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Abstract

In this thesis, we use the on-shell amplitude method to derive a loop-induced
amplitude without referring to a Lagrangian to determine the interaction
rules. As an example, we study Higgs production via gluon fusion, for which
we derive the amplitude for a subset of the contributing diagrams. This frame-
work therefore encodes, in a model-independent way, all possible beyond-the-
Standard-Model effects compatible with general principles such as Lorentz
invariance and little-group scaling of the amplitude. The amplitude obtained
is then matched onto its Standard Model Effective Field Theory (SMEFT)
counterpart, and complete agreement is found. The results of this thesis lay
the groundwork for systematically extending the on-shell amplitude approach
to the one-loop level, providing a general algorithm for the construction and
evaluation of loop amplitudes.
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Chapter 1

Introduction

The standard approach to compute scattering amplitudes relies on de-
termining the set of Feynman rules from the Lagrangian of a chosen theory.
These rules represent the basic building blocks for constructing scattering am-
plitudes and are conveniently expressed in terms of Feynman diagrams. Once
we specify the process of interest, we systematically enumerate all allowed
diagrams and sum them to obtain the corresponding scattering amplitude.
When the relevant couplings permit a perturbative treatment, we end up
with a power-series expansion in small coupling constants. The evaluation
of these diagrams becomes highly non-trivial when loop contributions are in-
volved, as we must deal with complicated integrals over the loop momenta
and we must also take into account the regularization and renormalization of
the theory [1–3].

The Standard Model (SM) of particle physics provides the theoretical
framework in which such calculations can be consistently performed. How-
ever, it is widely recognized as an incomplete theory since, for instance, it
fails to describe the mass of neutrinos, has no viable dark matter candidate
and cannot generate the excess of baryons over antibaryons in the universe.
Indeed, it is commonly interpreted as a low-energy effective description of an
unknown more fundamental ultraviolet (UV) theory. A systematic and model-
independent way to describe potential new physics is to extend the SM by
higher-dimensional operators, leading to a more general description known
as the Standard Model Effective Field Theory (SMEFT). In this approach,
we supplement the SM Lagrangian by an infinite tower of higher-dimensional
operators, each multiplied by a so-called Wilson coefficient whose structure
remains unknown. We construct these local operators using the SM fields
and asking to satisfy fundamental symmetry requirements, in particular in-
variance under the SM gauge group, SU(3)c × SU(2)L × U(1)Y , as well as
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2 Introduction

Lorentz invariance. Moreover, we take the fields to transform exactly as in
they do in the SM. The effects of heavy degrees of freedom, which are not di-
rectly accessible at current energies, are encoded into the Wilson coefficients,
suppressed by a characteristic energy scale Λ, associated with the scale of new
physics. In general an effective theory is valid in the regime where the typical
energy of the process satisfies E ≪ Λ [4,5].

Within this scheme, a key strategy to probe beyond-the-Standard-Model
(BSM) physics is to analyze experimental data collected at high-energy par-
ticle accelerators by performing fits to observables, such as cross sections,
computed in SMEFT. In particular, global fits are performed [6–9] for the
Wilson coefficients that can give a guideline on where new physics can show
up and how. These fits identify which deformations of SM interactions remain
experimentally allowed and help prioritize future measurements. The SMEFT
framework is though limited. Not only does it assume that new physics com-
pletely decouples, but also that the Higgs boson is part of an SU(2) doublet,
which is just an assumption and not an experimentally proven fact. The
so-called Higgs Effetive Field Theory (HEFT) relaxes the assumption of a
linearly realized Higgs doublet. The electroweak Goldstone bosons are de-
scribed nonlinearly, while the physical Higgs is treated as an independent
scalar singlet under the nonlinear realization. Its expansion is more compli-
cated and organized by an appropriate chiral or HEFT power counting [10,11].

In this context, the amplitude approach provides a robust framework that
can yield broader theoretical insights. In particular, the on-shell approach
parametrizes interactions directly in terms of amplitudes, without choosing an
off-shell operator basis. Its construction is instead organized by the assumed
particle content, symmetries, locality and power counting. This comes with
many advantages, namely that no SU(2) structure of the scalar fields need to
be assumed, it avoids ambiguities from field redefinitions and allows to write
down process-specific all-order expressions in the EFT.

The first step to implement the amplitude method is to identify the phys-
ical process one wishes to study. In this thesis, we focus on gluon-gluon
fusion into a Higgs boson, which represents the dominant Higgs production
mechanism at the LHC and can therefore be probed with high precision exper-
imentally. In the amplitude method we rely on more general arguments with
respect to using a specific BSM theory. The amplitude is indeed bootstrapped
from Lorentz invariance, little-group scaling, dimensional analysis, locality
arguments, symmetry considerations, and possible factorization properties.
Furthermore, the on-shell approach can describe both decoupling effects of
the SMEFT type and non-decoupling effects characteristic of HEFT, without
assuming that the Higgs belongs to a linearly realized electroweak doublet. In
the non-decoupling case, the low-energy expansion must be organized using
an appropriate HEFT or chiral power counting. Moreover, it avoids issues re-
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lated to field redefinitions and operator choices, as well as unphysical degrees
of freedom like ghosts or issues related to gauge fixing.

An important aspect of this construction is that we must specify the he-
licities of the external massless particles from the outset for the amplitude
method to work properly. As a consequence, the contribution of each helicity
configuration becomes naturally manifest at the amplitude level. Why is this
important? At the High Luminosity Large Hadron Collider (HL-LHC) due to
the large amount of data, we will be able to test kinematic features via multi-
dimensional distributions, where we might be sensitive precisely to effects that
carry helicity suppressions from non-interference with the SM. Furthermore,
we get more and more sensitive to measurements that really probe helicities
and polarisation, or spin correlations link in quantum observables [12,13].

In general, the amplitude method outlined above works remarkably well
at tree-level. At this order, in fact, scattering amplitudes display a relatively
simple analytic structure: as functions of the external momenta, they can be
characterised at most by the simple poles associated with the internal prop-
agators. Moreover, assuming locality, the residues at these poles factorize
into products of lower-point on-shell amplitudes, hence we can decompose
a generic tree-level amplitude into the sum of a factorizable part, obtained
by gluing lower-point amplitudes through factorization channels, and a non-
factorizable part, which is instead bootstrapped from the general arguments
mentioned above. The contact interaction of the amplitude can be naturally
written by making its Lorentz- and little-group structure manifest. To this
end, the spinor-helicity formalism is implemented, as it allows to write the
momenta and polarization vectors in terms of spinors whose transformation
properties under Lorentz- and little-group are well-defined. As a result of
this, the possible singularities of the amplitude are contained in the factoriz-
able piece, whereas the coefficients that parametrize the bootstrapped section
can only be polynomial functions of the Mandelstam variables, hence admit
a Taylor expansion in the relevant variables. The energy dimension of these
coefficients is determined through dimensional analysis which forces us to in-
troduce a cut-off scale that is can be chosen as the minimal energy at which
unitarity would be violated. This clearly establishes a connection between
the on-shell scattering amplitudes and EFTs: each coefficient in the ampli-
tude expansion would in fact be related to a certain combination of Wilson
coefficients of the chosen EFT [14].

What about loop corrections? In this case, the amplitudes are no longer
merely meromorphic functions of the external kinematics. Instead, they de-
velop a richer analytic structure, including branch cuts and logarithmic singu-
larities generated by loop integrations. These non-analytic features encode the
discontinuities of the amplitude and may be systematically studied through
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unitarity methods [15].

This thesis to our knowledge gives the first application of an agnostic
amplitude basis to the one-loop case, build on bootstrapped contact terms
and general on-shell htt̄ and gt̄t three-point structures. Accomplishing this
extension represents a major step forward, as it allows us not only cap-
ture the well-established SM contributions to a given amplitude, but also
to probe all possible Beyond-the-Standard-Model physics effects in a model-
independent way beyond tree-level. Qualitatively, the general procedure to
achieve this goal can be summarized in the following steps. We first construct
the model-independent one-loop amplitude starting from the relevant model-
independent tree-level lower-point amplitudes entering the process. This point
relies crucially on the implementation of both massless and massive spinor-
helicity formalism. Then, we expand this amplitude into a sum over the cho-
sen basis of scalar loop integrals, together with the rational term contribution,
each multiplied by an a priori unknown coefficient. Finally, by exploiting gen-
eralized unitarity techniques [15, 16], we determine the precise expression for
all these coefficients. In this last step, performing 4-dimensional cuts over the
internal propagators of the relevant Feynman diagrams of the process ensures
the determination of only the cut-constructible part of the amplitude. By
promoting the cuts to d dimensions [15,17], the rational term is also properly
captured. Needless to say, the resulting expression must contain the SM con-
tribution, providing a valuable and controlled benchmark for the calculation.

The thesis work is structured as follows. In Ch. 2 we summarize the main
problems of the SM of particle physics. We account for both experimental
and theoretical reasons. This is the starting point for the search for BSM
physics. Then, in Ch. 3 we review the traditional approach to probe BSM
physics. Hence, after briefly introducing the general grounds of EFTs, we
discuss SMEFT. We concentrate on the dimension-6 operators relevant for
the gg → h process in the Warsaw basis. Then, by means of SmeftFR
v3.03 [18–20], FeynArts [21], and FeynCalc [22–24], we reproduce the LO
SMEFT amplitude for the process of interest. We recover the result reported
in Ref. [25].

In Ch. 4, we introduce both the massless and massive spinor-helicity for-
malisms. We adopt a hands-on approach by providing some relevant exam-
ples. The aim of this chapter is to establish the power of little-group transfor-
mations in deriving on-shell tree-level amplitudes in a bottom-up approach.
Then, in Ch. 5 we specialize this technology to evaluate the tree-level on-shell
amplitude for the process hgg, as well as those for htt̄ and t̄tg. These latter
two amplitudes are the building blocks for evaluating the one-loop gg → h
diagrams.

In order to move from tree-level to one-loop amplitude methods, in Ch. 6
we review the main amplitude techniques to compute one-loop amplitudes
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and establish the connection with generalized unitarity. In this context, we
introduce the van Neerven–Vermaseren basis, which can be implemented to
efficiently reconstruct an amplitude by performing unitarity cuts.

Finally, in Ch. 7 we have all the tools required to perform the calculation
of one-loop Higgs production via gluon fusion. For the scope of this thesis,
we perform the calculation considering the two SM-like diagrams with top
quarks circulating in the loops. We first simplify the evaluation by bench-
marking the algorithm against the SM contribution, which is correctly repro-
duced. We then promote the approach to the BSM structures at first order
in the 1/Λ expansion. Here, generalized unitarity methods are implemented
computationally by means of Mathematica [26] and its interface with the
package SMaSH [27]. Finally, we provide the matching of the amplitude we
obtain with the one derived in the SMEFT framework. The correct imple-
mentation of the amplitude method allows this matching to work properly.
Finally, Ch. 8 provides a summary and outlook.





Chapter 2

Motivations for physics beyond
the Standard Model

Although the SM has been extremely successful in describing a wide range
of experimental data, there are several reasons to believe that it cannot be
the final theory of fundamental interactions [28]. These motivations can be
divided into experimental observations and theoretical considerations.

2.1 Experimental reasons

• Neutrino masses and oscillations. In the SM, neutrinos are massless
particles. This is because of the restricted particle content of the SM: it
does not contain right-handed neutrino fields, and therefore neutrinos
cannot acquire a Dirac mass through the Higgs mechanism. However,
neutrino oscillation experiments have shown that neutrinos produced
in a given flavor state can change their flavor during propagation [29,
30]. This implies that the flavor eigenstates do not coincide with the
propagation eigenstates, namely the mass eigenstates. It turns out that
neutrinos are much lighter than the other SM fermions, suggesting that
their masses may originate from a different mechanism. Moreover, the
ordering of the neutrino mass eigenstates is still under investigation and
is usually referred to as the neutrino mass ordering.

Different solutions have been proposed in order to give mass to neutri-
nos. A minimal extension of the SM consists in adding right-handed
neutrinos and Yukawa interactions, so that neutrinos acquire a mass
through the Higgs mechanism. We consider the right-handed neutrinos
as singlets under SU(3)c × SU(2)L × U(1)Y , hence they are sterile and
can only be probed indirectly. So far, no conclusive evidence for right-
handed neutrinos has been found. Moreover, following this strategy,
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8 Motivations for physics beyond the Standard Model

we end up with an exceedingly small Yukawa coupling, especially when
compared to the top Yukawa coupling.

Another possibility is that neutrinos are Majorana particles. In the
minimal SM, this possibility is forbidden by the lepton-number conser-
vation which emerges as an accidental global symmetry of theory. In
particular, the see-saw mechanism introduces a heavy right-handed Ma-
jorana neutrino which is still sterile under the SM gauge group. This
time, however, we are able to provide a small mass to the neutrinos
without assuming an unnaturally small value of the Yukawa coupling.
From an experimental point of view, if neutrinos are Majorana particles,
neutrinoless double-β decay provides a possible probe. The observation
of this process would therefore establish lepton-number violation and,
under very general assumptions, imply a Majorana mass component for
neutrinos.

• Dark matter. Galaxy rotation curves and gravitational lensing obser-
vations suggest the existence of a form of matter that interacts gravita-
tionally but is invisible to electromagnetic radiation. This component is
known as dark matter and accounts for approximately 84% of the total
matter content of the Universe [31].

In terms of particles, the SM does not provide a viable candidate for
dark matter. In particular, the only SM particles with the right qual-
itative features are neutrinos, since they are neutral and weakly inter-
acting. However, their small masses make them relativistic at decou-
pling and until late times, corresponding to hot dark matter. Their free
streaming out of gravitational potential wells suppresses the formation
of structures on small scales, making them incompatible with the ob-
served large-scale structure if they constituted all of the dark matter.
They can therefore account for only a small fraction of the observed
dark matter relic density. Therefore, a particle-physics explanation of
dark matter requires new degrees of freedom beyond the SM.

• Matter–antimatter asymmetry. It is known that the observable
Universe contains much more matter than antimatter. In order to dy-
namically generate such an asymmetry, the Sakharov conditions must
be satisfied: baryon-number violation, C and CP violation, and a depar-
ture from thermal equilibrium [32]. In this regards, the amount of CP
violation introduced by the minimal SM is not sufficient. Therefore, the
SM cannot account for the observed baryon asymmetry of the Universe.
This suggests the presence of additional sources of baryon-number vio-
lation and CP violation, together with a new mechanism for departure
from thermal equilibrium, beyond the SM.
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2.2 Theoretical reasons

• Naturalness and the hierarchy problem. One of the main theo-
retical motivations for physics beyond the SM is the hierarchy between
the electroweak scale and much higher energy scales. In particular, the
SM may remain valid up to energies close to the Planck scale,

ΛPl ∼ 1019GeV,

while electroweak symmetry breaking occurs at the much lower scale

v ≃ 246GeV.

The Higgs sector is particularly sensitive to this large separation of
scales. Because the Higgs mass parameter is not protected by a sym-
metry, particles at a heavy scale M that couple to the Higgs generally
induce corrections proportional to M2. If such scales are far above
the electroweak scale, obtaining v ≃ 246 GeV can require cancellations
among independent contributions. This requires a large amount of fine
tuning among various contributions which ask for an explanation. This
sensitivity is the electroweak hierarchy or naturalness problem.

• Triviality and vacuum stability. The Higgs sector may also develop
problems when the SM is extrapolated to very high energies. In partic-
ular, the Higgs self-interaction changes with the energy scale because of
quantum effects. For present central values of the Higgs and top-quark
masses and the strong coupling constant, high-order SM calculations
typically place the electroweak vacuum in the metastable region, with a
tunnelling lifetime vastly longer than the age of the Universe. The dis-
tinction between absolute stability and metastability remains sensitive
to the above-mentioned parameters [33].

• The cosmological constant problem. Another important theoreti-
cal problem concerns the extremely small observed value of the cosmo-
logical constant. The vacuum-energy density inferred from cosmological
observations is tiny compared with the values we would naturally ex-
pect from the energy scales of particle physics, and even more so when
compared with the Planck scale. The enormous difference between the
observed value and theoretical expectations represents one of the most
striking hierarchy and naturalness problems in fundamental physics.

• Unexplained flavor structure. The SM successfully describes the
masses and interactions of quarks and leptons, but it does not explain
why these parameters take the values observed in nature. Fermion
masses span a very wide range, and the patterns of mixing among quarks
and leptons are also remarkably different. These quantities are intro-
duced in the SM as free parameters determined experimentally. The
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origin of this flavor structure therefore remains unexplained and may
point toward additional symmetries, interactions, or organizing princi-
ples beyond the SM.

• Strong CP problem. At the renormalizable level, the SM Lagrangian
must contain the term

LSM ⊃ θ
g2s

32π2
Ga,µνG̃a

µν , (2.1)

with θ being a dimensionless parameter, and G̃a
µν = 1

2ϵµνρσG
a,ρσ. This

operator violates CP in the QCD sector of the SM Lagrangian. In
particular, measurements of the electric dipole moment of the neutron
lead to the bound |θ| ≲ 10−10 [34], implying that CP violation in the
strong interactions is extremely small. The exceedingly small value of
θ is known as the strong CP problem.

Many possible solutions to these problems have been proposed, including
new particles, new symmetries, new interactions, unification mechanisms, and
extended Higgs sectors. However, no direct evidence for a specific BSM model
has been found so far. For this reason, effective field theories provide a useful
framework to describe possible new-physics effects [35,36], if the new physics
is assumed to be much heavier than the electroweak scale. We present the
groundwork of EFTs in the next chapter.



Chapter 3

Effective field theories as tools
to probe BSM physics

Effective Field Theories (EFTs) provide a general framework to describe
the physics of a system at a given energy scale without requiring the full
knowledge of its dynamics. The basic idea is that, if one is interested in
processes occurring at energies much smaller than a certain high-energy scale
Λ, the details of the dynamics above Λ do not need to be known explicitly. We
encode their effects in a systematic expansion in powers of small parameters,
such as E/Λ or m/Λ, where E is the typical energy of the process and m
denotes a light mass scale [37–41].

An EFT must be constructed in such a way to fulfill the general require-
ments of the system under study, such as its symmetries. In this sense, an
EFT is the most general field theory describing the relevant low-energy de-
grees of freedom, which is organized according to a given power counting
prescription. More explicitly, an EFT is specified by:

• the set of light fields, together with their transformation properties un-
der the symmetries of the system;

• the symmetries that determine which interactions are allowed;

• a power-counting rule, which organizes the Lagrangian as an expansion
in small parameters.

In principle an EFT receives contributions from an infinite tower of higher-
dimensional operators. Hence, how can such a theory be predictive? In
general only a finite number of them contributes at any fixed order in the
expansion. Therefore, physical observables can be computed to a given preci-
sion in terms of a finite number of parameters, which can either be measured
experimentally or derived from a more fundamental theory.

11



12 Effective field theories as tools to probe BSM physics

3.1 Top-down and bottom-up approaches

In QFT, we typically use Lagrangians to encode the behaviour of a theory.
In this context, an EFT Lagrangian acts as a bridge between a high-energy
theory and low-energy observables. This connection can be used in two com-
plementary ways.

Top-down approach. In the top-down approach, one starts from a known
ultraviolet theory and derives the corresponding low-energy EFT. Suppose
that the full theory contains light fields ϕℓ, with masses mℓ ≪ Λ, and heavy
fields ϕh, with masses mh ≳ Λ. The ultraviolet theory can be schematically
written in terms of an action of fields

SUV(ϕℓ, ϕh) =

∫
d4xLUV(ϕℓ, ϕh, c), (3.1)

where c parametrizes the coupling constants of the high-energy theory.
Therefore, the generating functional of the full theory reads

ZUV[Jℓ, Jh] =

∫
DϕℓDϕh exp

[
i

(
SUV(ϕℓ, ϕh) +

∫
d4xJℓϕℓ +

∫
d4xJhϕh

)]
,

(3.2)
where Jℓ and Jh are the light and heavy external sources, respectively.

Conversely, the low energy theory can be described by an action of light
fields only

SIR(ϕℓ) =

∫
d4xLIR(ϕℓ, c

′). (3.3)

Notice that the Lagrangian depends on specific IR parameters, denoted with
c′, which are commonly referred to as Wilson coefficients. The path integral
of this theory can be straightforwardly written as

ZIR[Jℓ] =

∫
Dϕℓ exp

[
i

(
SIR(ϕℓ) +

∫
d4xJℓϕℓ

)]
, (3.4)

where the heavy external source has been switched off. Now, since in the IR
region the two theories must give the same predictions, this implies

ZIR[Jℓ] = ZUV[Jℓ, Jh = 0]. (3.5)

This relation means that, since the heavy fields cannot be produced on-shell
in the low energy theory, they are removed from the complete spectrum by
integrating them out. It is enough to require that

eiSIR(ϕℓ) ≡
∫

Dϕh e
iSUV(ϕℓ,ϕh), (3.6)

in order to guarantee the above relation. We define the Wilsonian action as

SW(ϕℓ) ≡ SIR(ϕℓ), (3.7)
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which governs the low energy behaviour of the light fields.
In general, the task of determining this action is not trivial. Integrating

out the heavy fields gives, in general, a non-local description. However, at
energies much smaller than the heavy scale, E ≪ Λ, the effects associated
with the heavy degrees of freedom admit an expansion in powers of 1/Λ.
This can be seen straightforwardly at tree level. For instance, the propagator
of a heavy particle can be expanded as

1

p2 − Λ2
= − 1

Λ2

(
1 +

p2

Λ2
+
p4

Λ4
+ · · ·

)
, p2 ≪ Λ2, (3.8)

so that the exchange of the heavy particle is reproduced by a tower of lo-
cal interactions with increasing numbers of derivatives. A similar argument
applies at loop level, see e.g., [42]. Therefore, at low energies, the effects of
the heavy degrees of freedom can be encoded in a local expansion in inverse
powers of the heavy scale. The corresponding EFT Lagrangian can then be
written as

LIR(ϕℓ, c
′) =

∑
n

L
(n)
IR (ϕℓ, c

′), (3.9)

where each term contains the appropriate power of 1/Λ. The procedure that
determines the low-energy Wilson coefficients c′ by comparing the UV theory
and the EFT is called matching.

After matching, the Wilson coefficients are evolved from the high scale
down to the low-energy scale at which measurements are performed. This evo-
lution is governed by renormalization-group equations and is called running.
Finally, the EFT is used to compute physical observables at low energies.

Bottom-up approach. In the bottom-up approach, the ultraviolet theory
is not specified. Instead, one constructs the most general low-energy La-
grangian compatible with the known degrees of freedom and symmetries. For
example, if Lorentz invariance and gauge invariance are imposed, all operators
consistent with these symmetries must be included.

The bottom-up EFT therefore takes the form

LIR(ϕℓ, c
′) =

∑
n

L
(n)
IR (ϕℓ, c

′), (3.10)

where the expansion is organized according to the chosen power-counting rule,
and as before, the required precision determines where the expansion has to
be truncated. In this case however, the Wilson coefficients are treated as free
parameters and are constrained by experimental data.

This approach is particularly useful when the underlying high-energy the-
ory is unknown, or when matching from the UV theory is too difficult to
perform explicitly. In particular, a bottom-up approach is usually employed
to parametrize BSM physics. In EFT approaches to new physics, the SM
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is augmented with higher-dimensional operators compatible with the sym-
metries of the theory. In this case the low-energy fields are the SM fields
themselves and local interactions are required.

In this context, the scale of new physics, as well as the pattern and relative
size of the Wilson coefficients associated with the different effective operators,
are among the big open questions in particle physics. In the next section, we
will provide a parametrization of BSM physics by means of SMEFT.

We should briefly comment on the role of field redefinitions in an EFT
Lagrangian. In particular, the S-matrix equivalence theorem states that S-
matrix elements do not depend on the choice of interpolating fields [43]. They
are indeed invariant under local field redefinitions. This can be understood
from the LSZ reduction formula, which relates momentum-space Green’s func-
tions to physical S-matrix elements [2]. Although field redefinitions can mod-
ify the Green’s functions and their residues, these changes do not affect the
resulting S-matrix elements. This allows us to employ the equations of mo-
tion of the fields to eliminate redundant operators in the EFT expansion.
This point is particularly important since, at a fixed order in the expansion
of an EFT Lagrangian, some of the operators that we would naively write in
a bottom-up approach may instead be related by field redefinitions. This is,
in general, a non-trivial task and requires fixing a basis of operators to work
with. More on this will be provided in the context of the SMEFT operators.

3.1.1 Power counting

As discussed above, we need a rule that allows us to organize the EFT
expansion. This is known as power counting. Qualitatively, it dictates which
operators must be kept at a given order [43]. More explicitly, consider a
scattering amplitude normalized to have mass dimension zero. If the relevant
energy scale of the process is E, the insertion of a single operator of dimension
n > 4 gives a contribution of order

M ∼
(
E

Λ

)n−4

. (3.11)

Here, it is assumed that all the relevant light kinematic scales are of order
E and that no additional suppressions are present. This follows from di-
mensional analysis, since the coefficient of a dimension-n operator has mass
dimension 4− n and is therefore suppressed by Λn−4.

More generally, if several higher-dimensional operators are inserted, the
amplitude scales as

M ∼
(
E

Λ

)N

, (3.12)

where
N =

∑
i

(ni − 4) , (3.13)
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and the sum runs over all inserted operators.
This formula shows how the EFT expansion is organized when the power

counting is based on the canonical dimension of the operators, as in SMEFT
[43]. Other EFTs may require a different power counting scheme. For in-
stance, in HEFT the loop expansion also enters the power counting [10]. At
leading order one keeps only the renormalizable part of the Lagrangian which
is given by operators of dimension equal or lower to n. Corrections of order
E/Λ instead arise from one insertion of a dimension-five operator. Correc-
tions of order (E/Λ)2 can arise either from one insertion of a dimension-six
operator or from two insertions of dimension-five operators, and so on.

The same logic applies at loop level. For instance, if a loop diagram
with two insertions of dimension-five operators is divergent, the correspond-
ing counterterm has the structure of a dimension-six operator. This reflects
the fact that EFTs are non-renormalizable in the traditional sense: renormal-
ization requires an infinite tower of higher-dimensional operators.

Fortunately, this does not spoil predictivity. At any fixed accuracy in the
expansion, only a finite number of operators contributes. Therefore, we can
use EFTs as well-defined and predictive framework for describing low-energy
phenomena without knowing the detailed dynamics at energies of order Λ or
above.

3.2 SMEFT

Up to now, we have provided the basic tools for understanding the EFT
framework without relying on a specific theory. In this section, we use this
technology to describe BSM effects in SMEFT.

SMEFT provides a model-independent description of possible deviations
from the Standard Model at energies below the characteristic scale of new
physics which we still call Λ. As for the general case, the main assumption
is that the high-energy effects are encoded by significantly heavier degrees of
freedom with respect to those at the electroweak scale. This means that the
former can be integrated out. This results in an expansion encoded in a tower
of higher-dimensional local operators constructed exclusively from Standard
Model fields and invariant under the gauge SM group

SU(3)c × SU(2)L × U(1)Y . (3.14)

In SMEFT, the Higgs field is assumed to belong to an SU(2)L doublet, so
that electroweak symmetry breaking is linearly realized as in the Standard
Model.

The SMEFT Lagrangian is obtained exploiting a bottom-up approach,
and is organized as an expansion in inverse powers of the new-physics scale
Λ,

LSMEFT = LSM +
∑
d>4

L(d), L(d) =
∑
i

C
(d)
i

Λd−4
Q

(d)
i , (3.15)
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where LSM is provided in Appendix A.1, Q
(d)
i are gauge-invariant operators

of dimension d, while C
(d)
i are the corresponding Wilson coefficients. These

parametrize the high-energy content which has been integrated out from the
unknown ultraviolet (UV) completion. These coefficients are taken to be
dimensionless since their mass dimension is made explicit via the Λ parameter.

In this work we focus on dimension-six operators only, and use the first
non-redundant operator basis determined in the literature, namely the so-
called Warsaw basis [44]. The construction of this basis was achieved by
making field redefinitions on the SM fields, use integration by parts identities
as well as Fierz identities. In particular, The Warsaw basis is constructed
such as to remove as many derivative operators as possible. Clearly, as al-
ready pointed out many field redefinitions are possible and one should fix a
preferable one from the outset. More on this can be found in [45].

We do not attempt a comprehensive review of SMEFT here. Instead, we
retain only the dimension-6 operators relevant to the analysis of Higgs produc-
tion through gluon fusion, which is the main production mode at the LHC. In
particular, the SM contribution to this process is loop induced, and, at lead-
ing order, the dominant contribution is generated by a top-quark triangle. In
SMEFT, this process receives both modifications of the top-mediated ampli-
tude and genuinely new contributions. In principle, loops involving lighter
quarks may also contribute in SMEFT, however, in the following we restrict
our analysis to the top-quark contribution and neglect light-quark loops. The
operators that directly generate the relevant interaction structures are [20]

QφG =
(
φ†φ

)
Ga

µνG
aµν ,

Q
φG̃

=
(
φ†φ

)
Ga

µνG̃
aµν ,

Q33
uG = (q̄3σ

µνT atR) φ̃ G
a
µν ,

Q33
uφ =

(
φ†φ

)
(q̄3tRφ̃) ,

Qφ□ =
(
φ†φ

)
□
(
φ†φ

)
,

QφD =
(
φ†Dµφ

)∗ (
φ†Dµφ

)
.

(3.16)

where

φ̃ = iσ2φ
∗, G̃a

µν =
1

2
ϵµνρσG

aρσ, (3.17)

q3 = (tL, bL)
T is the third-generation left-handed quark doublet, and the

covariant derivative is defined in Eq. (A.7).
Therefore, we are interested in the following part of the SMEFT La-
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grangian

L
(6)
SMEFT ⊃ 1

Λ2

[
CφGQφG + C

φG̃
Q

φG̃

+
(
C33
uGQ

33
uG + C33

uφQ
33
uφ + h.c.

)
+ Cφ□Qφ□ + CφDQφD

]
.

(3.18)

Here, the coefficients CφG and C
φG̃

are real. These two operators are respon-
sible for the non-vanishing tree level amplitude for gg → h, which is absent
in the SM case. CφG produces a CP-even interaction, whereas C

φG̃
produces

its CP-odd counterpart.
The latter four operators in the list contribute only to the loop diagrams.

The first one, Q33
uG, provides a genuinely new contribution by modifying the

top-gluon vertices and is usually referred to as the chromomagnetic dipole
operator. The remaining three operators modify the top-Higgs interaction.
In particular, Qφ□, QφD, and Re

(
Q33

uφ

)
modify the CP-even top Yukawa

coupling, while a non-zero Im
(
Q33

uφ

)
generates a CP-odd pseudoscalar top-

Higgs interaction. Consequently, the Higgs coupling to top quarks contains
both CP-even and CP-odd components, leading to CP violation.

In Appendix A.2, we first provide the relevant Feynman rules for the
process gg → h at one loop. Then, we summarize the steps required to obtain
computationally the SMEFT amplitude at leading order (LO) in the EFT
expansion, i.e. at O(1/Λ2). Considering the CP-even part of the amplitude,
we obtain

MSMEFT(g(p1) + g(p2) → h) = i
αs

3πv
δab ε1µε2ν [p

ν
1p

µ
2 − (p1 · p2)gµν ]F (τ),

(3.19)
with

F (τ) = ctF1(τ) + cg(µR)F2(τ) + Re(ctg)
m2

v2
F3(τ). (3.20)

The expressions for the coefficients ct, cg, and ctg in terms of the Wilson
coefficients are given in Eq. (A.32), whereas the form factors F1(τ), F2(τ),
and F3(τ) are given in Eq. (A.31), with τ ≡ 4m2/m2

h and m the top mass.
The above result coincides with that of Ref. [25].





Chapter 4

The on-shell way

Effective field theories, such as SMEFT and HEFT, provide a system-
atic way to parametrize the unknown effects of physics beyond the Standard
Model. However, they unavoidably rely on the assumptions made when con-
structing the Lagrangian. A possible way to describe BSM effects without
relying on a specific BSM Lagrangian, is to use on-shell amplitude methods.
In this framework, the fundamental object is the scattering amplitude itself
rather than the Lagrangian, which is not explicitly specified. These ampli-
tudes can be constructed by relying on general principles such as Lorentz
invariance, little-group scaling, and locality.

In this section, we introduce the spinor-helicity formalism, which provides
the mathematical language needed to parametrize model-independent on-shell
amplitudes. Both the massless and massive versions of the formalism are
discussed, together with some useful examples that establish the notation
and illustrate the underlying working principles.

4.1 The massless spinor helicity formalism

The spinor-helicity formalism is commonly employed in the calculation of
scattering amplitudes. Compared to the conventional four-vector formalism,
it has several advantages, as it makes the helicity structure of an amplitude
manifest from the outset. In the case of massless particles, helicity is conserved
under free time evolution and is also invariant under Lorentz transformations.
It therefore serves as a quantum number that labels an irreducible represen-
tations of the Poincaré group. For this reason, it is convenient to start from
the massless case, where the formalism is more naturally defined, and then
extend it to the massive case.

We begin the discussion with Dirac spinors and later extend it to spin-1
particles. In Appendix B, we introduce the notation used in this section.

19
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By reviewing the representations of the Lorentz group, we introduce left-
and right-handed spinors as the objects of its first two non-trivial irreducible
representations. We denote by D(jL,jR) the (2jL + 1)(2jR + 1)-dimensional
representation of the Lorentz group, where jL and jR label the representations
associated with the two independent SU(2) algebras introduced in Eq. (B.11).
Therefore, we denote by

D( 1
2
,0) and D(0, 1

2
), (4.1)

the left- and right-handed Weyl representations, respectively. These repre-
sentations act on left-handed spinors ψa(x) and right-handed spinors ψ†

ȧ(x),
respectively. Here, undotted and dotted indices each take two values, since
both representations are two dimensional. By convention, undotted indices
transform in the left-handed representation, while dotted indices transform
in the right-handed one. In this context, a Dirac field is a four-dimensional
completely reducible representation of the Lorentz group, given by

DDirac = D( 1
2
,0) ⊕D(0, 1

2
). (4.2)

On the other hand, the vector representation is provided by their tensor prod-
uct,

D( 1
2
, 1
2
) = D( 1

2
,0) ⊗D(0, 1

2
). (4.3)

This is a 4-dimensional irreducible representation of the Lorentz group. In
fact, although under rotations only the spatial components of a four-vector
are mixed, the presence of boosts ensures that all components are mixed with
each other. A natural question arises: are we sure that this is actually the
Lorentz vector representation? The other possible candidates may be the
representations (32 , 0) and (0, 32), which have the correct dimension. However,
these two contain only angular momentum j = 3

2 , whereas (12 ,
1
2) contains

j = 0 and j = 1, which coincides with the behavior of a Lorentz vector under
rotations. This property allows us to make a general statement about the
structure of a Dirac field.

Consider a field carrying one undotted and one dotted index, Aaȧ(x). Such
a field belongs to the

(
1
2 ,

1
2

)
representation, namely to the Lorentz vector rep-

resentation. A field in the vector representation is usually written as Aµ(x),
where µ is a Minkowski index. Therefore, there must exist a dictionary relat-
ing the components of Aaȧ(x) to those of Aµ(x). This relation can be written
as [3]

Aaȧ(x) = σµaȧAµ(x), (4.4)

and analogously
Aȧa(x) = σ̄µ ȧaAµ(x), (4.5)

where the symbols σµaȧ and σ̄µ ȧa contain the Pauli matrices and are defined
in Eqs. (B.31) and (B.34).
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We specialize the two relations above to the case of a momentum four-
vector, since we generally work in momentum space:

pµ =
(
p0, pi

)
=
(
E, pi

)
, pµpµ = m2. (4.6)

By contracting it with the gamma matrices in the chiral-basis representation
of Eq. B.40, we can write

/p =

(
0 paȧ
p̄ȧa 0

)
, (4.7)

with

paȧ ≡ pµ (σ
µ)aȧ =

(
p0 − p3 −p1 + ip2

−p1 − ip2 p0 + p3

)
, (4.8)

and similarly
p̄ȧa ≡ pµ (σ̄

µ)ȧa . (4.9)

The momentum bispinors paȧ and p̄
ȧa can be regarded as 2×2 matrices. Their

determinant is Lorentz invariant and satisfies

det p = pµpµ = m2. (4.10)

4.1.1 Spinor notation

The momentum-space Dirac equation reads(
/p−m

)
u(p) = 0 and

(
/p+m

)
v(p) = 0. (4.11)

Here, u(p) and v(p) denote the Dirac wave functions in momentum space,
linear combinations of which form a Dirac field,

Ψ(x) ∼ u(p)e−ip·x + v(p)eip·x, (4.12)

which satisfies the Dirac equation in coordinate space. To work in the chiral
representation, which distinguishes left- and right-handed representations, we
introduce the chirality projectors

P± =
1 ± γ5

2
, (4.13)

with γ5 = iγ0γ1γ2γ3. Here, we consistently employ the chiral representation
of the gamma matrices provided in Appendix B.1.1.

We now label the left- and right-handed representations by ±, referring to
the two possible values of the helicity of the fermionic particle, h = ±1

2 . This
can be done, since we consider for now the massless limit, in which chirality
and helicity coincide. In our notation, chirality is actually opposite to helicity
only for antiparticles, as is evident in Eqs. (4.14) and (4.15). In the massless
case, helicity becomes a Lorentz-invariant quantity.
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h > 0 h < 0

E > 0

ū+

p
u+

ū−

p
u−

E < 0

v+

p
v̄+

v−

p
v̄−

Table 4.1: Relation between the sign of the energy, helicity, and the corresponding
chiral spinors. The yellow arrow indicates the spin direction, while the red arrow
indicates the momentum direction.

As mentioned above, a massless particle is completely specified by its
helicity and by the sign of its energy, since [Ĥ, ĥ] = 0, where Ĥ is the Dirac
Hamiltonian and ĥ is the helicity operator. In this context, u(p) represents
positive-energy solutions, while v(p) represents negative-energy solutions. We
further specify their chirality and helicity by defining the chiral spinors as

u±(p) = P±u(p), v∓(p) = P±v(p), (4.14)

ū±(p) = ū(p)P∓, v̄∓(p) = v̄(p)P∓. (4.15)

In Tab. 4.1, we provide a diagrammatic representation of the chiral spinors
and their Dirac adjoints. Each spinor is identified by its helicity and by the
sign of its energy. The yellow arrows represent the direction of the spin,
whereas the red arrows represent the momentum flow, which is conventionally
chosen from left to right.

Moreover, crossing symmetry, namely incoming ↔ outgoing and fermions
↔ antifermions, exchanges the wave functions and flips the sign of the helicity.
Therefore, in the massless case the wave functions are related as

u± = v∓ and v̄± = ū∓. (4.16)

The last step is to introduce an explicit representation of the wave func-
tions. This is done in terms of angle and square spinors, which are the central
objects of the spinor-helicity formalism:

u+(p) = v−(p) =

(
0

|p]ȧ
)
, u−(p) = v+(p) =

(
|p⟩a
0

)
,

ū+(p) = v̄−(p) =
(
⟨p|a 0

)
, ū−(p) = v̄+(p) =

(
0 [p|ȧ

)
.

(4.17)

These spinors must satisfy the massless Dirac equation in momentum space,
namely

/p u±(p) = /p v±(p) = ū±(p)/p = v̄±(p)/p = 0; (4.18)
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this requires the angle and square spinors to satisfy

p̄ȧa|p⟩a = 0, paȧ|p]ȧ = 0, [p|ȧp̄ȧa = 0, ⟨p|apaȧ = 0, (4.19)

where the representation of /p in Eq. (4.7) has been used. These equations are
the massless Weyl equations.

4.1.2 Properties of angle and square spinors

In this section we present the main properties of the angle and square
spinors which will be necessary for later applications.

Reality conditions. The Dirac-conjugate field Ψ̄ is obtained from Ψ by
Dirac conjugation. When this operation is applied to the momentum-space
Dirac equations, it relates the spinors associated with particles and antipar-
ticles. This relation, however, holds only if the momentum pµ is real, namely
if all its components are real numbers. In that case, angle and square spinors
are not independent, but are related by complex conjugation:

pµ ∈ R : (|p⟩a)∗ = [p|ȧ,
(
|p]ȧ
)∗

= ⟨p|a. (4.20)

For complex momenta, instead, this reality condition is lost; in this case,
angle and square spinors must be treated as independent variables. Let us
verify the first equality as a consistency check. Using the definition of the
Dirac adjoint and the γ0 defined in Eq. (B.40), we obtain

ū+(p) = u†+(p)γ
0

=
(
0
(
|p]ȧ
)∗)(0 1

1 0

)
=
((
|p]ȧ
)∗

0
)
.

(4.21)

On the other hand, from Eq. (4.17),

ū+(p) =
(
⟨p|a 0

)
. (4.22)

Comparing the two expressions, we find(
|p]ȧ
)∗

= ⟨p|a, (4.23)

as required.

Completeness relation. Consider the spin-sum completeness relations for
Dirac’s wavefunctions∑

h=±
uh(p)ūh(p) = /p,

∑
h=±

vh(p)v̄h(p) = /p, (4.24)
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where we have set m = 0. By employing the explicit forms of the chiral wave
functions in Eq. (4.17) and of /p in Eq. (4.7), we obtain

paȧ = |p⟩a[p|ȧ, p̄ȧa = |p]ȧ⟨p|a. (4.25)

These two expressions are 2 × 2 matrices that occupy the two off-diagonal
blocks of a larger 4× 4 matrix. For this reason, we can employ the following
abuse of notation, which will be used extensively in what follows:

/p ≡ |p⟩[p|+ |p]⟨p| (4.26)

where the 4× 4 matrix /p is written as the sum of its two 2× 2 components.
Notice we have also suppressed the Weyl indices.

Angle and square spinor brackets. Given two massless momenta p and
q, we define the Lorentz-invariant spinor products

⟨pq⟩ ≡ ⟨p|a|q⟩a, [pq] ≡ [p|ȧ|q]ȧ, (4.27)

where we have introduced the NW–SE ↘ contraction rule for undotted Weyl
indices and the SW–NE ↗ contraction rule for dotted Weyl indices. Since
the spinor indices are contracted with the two-component Levi-Civita ten-
sors ϵab and ϵȧḃ defined in Eq. (B.25), these products are antisymmetric by
construction

⟨pq⟩ = −⟨qp⟩, [pq] = −[qp]. (4.28)

Moreover,

⟨pp⟩ = 0, [pp] = 0. (4.29)

In case of mixed contractions between angle and square spinors, they do not
define Lorentz scalars, because they carry different types of spinor indices. In
this sense, one writes

⟨p|q] = ⟨p|a|q]ȧ = 0, [p|q⟩ = [p|ȧ|q⟩a = 0. (4.30)

More precisely, these expressions are not allowed scalar contractions unless an
object carrying one dotted and one undotted index, such as σµaȧ, is inserted.
We will address this point later.

A very useful identity relates spinor products to the scalar product of the
two momenta:

⟨pq⟩[qp] = 2p · q = (p+ q)2, (4.31)
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where in the last passage we used that the particle is massless. This relation
can be proved in the following way

⟨pq⟩[qp] = ⟨p|a|q⟩a [q|ȧ|p]ȧ

= p̄ȧaqaȧ

= pµ (σ̄
µ)ȧa qν (σ

ν)aȧ
= pµqν Tr(σ̄

µσν)

= 2pµqνg
µν

= 2p · q, (4.32)

where we used Eqs. (4.25), (4.8), (4.26) and (B.36).

Moreover, we adopt the following convention for negative spinor momenta

| − p⟩ = −|p⟩, | − p] = +|p]. (4.33)

Momentum conservation. In amplitude calculations, we use the all-incoming
convention, so that momentum conservation for an n-particle process reads

n∑
i=1

pµi = 0. (4.34)

In the spinor-helicity formalism this condition can be written by contract-
ing the momentum-conservation equation with arbitrary massless reference
spinors ⟨q| and |k]. Using the spinorial representation of a massless momen-
tum, one obtains

n∑
i=1

⟨qi⟩[ik] = 0, (4.35)

for any lightlike momenta q and k. This form is often very useful because it
allows to rewrite spinor products using momentum conservation directly.

Spinor bilinears. In amplitude calculations it is common to deal with
spinor bilinears which are constructed employing Pauli matrices in such a
way to properly contract all dotted and undotted indices.

With a similar notation abuse implemented in Eq. (4.108) we can write the
4-dimensional gamma matrices as the sum of its 2-dimensional Pauli matrices
components

γµ ≡ σµ + σ̄µ, (4.36)

in accordance with Eq. (B.40). With this object we can build spinors bilinears
like

[k|γµ|p⟩ and ⟨k|γµ|p], (4.37)

with kµ and pµ two different massless momenta. Note these expressions com-
bine the 2-component spinors with the 4 × 4 gamma matrices. We interpret
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these expressions thinking that the 2-component spinors act as projectors
which single out the matching sigma-matrix contained in γµ. Explicitly we
have

[k|γµ|p⟩ ≡ [k|ȧ (σ̄µ)ȧa |p⟩a and ⟨k|γµ|p] ≡ ⟨k|a (σµ)aȧ |p]ȧ. (4.38)

Some useful relations hold for spinors bilinears:

• Momentum reconstruction:

⟨k|γµ|k] = 2kµ. (4.39)

Contracting both sides with an arbitrary four-vector qµ, we find

qµ⟨k|γµ|k] = ⟨k|/q|k]
= ⟨k|q⟩[q|k]
= 2kµqµ. (4.40)

• Same-chirality contractions:

⟨p|γµ|k⟩ = 0, [p|γµ|k] = 0. (4.41)

Following the discussion we have just presented, it is not possible in this
case to project the γ-matrix onto a Pauli-matrix whose indices contract
consistently with the spinors. In particular

⟨p|γµ|k⟩ = ⟨p|a (σµ)aȧ |k⟩a, [p|γµ|k] = [p|ȧ (σ̄µ)ȧa |k]ȧ. (4.42)

In both cases, one spinor index remains of the wrong type, so no Lorentz-
covariant contraction can be formed. Hence these same-chirality con-
tractions vanish.

• Charge conjugation:

[k|γµ|p⟩ = ⟨p|γµ|k]. (4.43)

Contracting both sides with an arbitrary four-vector qµ, we find

qµ[k|γµ|p⟩ = [k|/q|p⟩
= [k| (|q]⟨q|) |p⟩
= [kq]⟨qp⟩
= [qk]⟨pq⟩
= ⟨p|/q|k]
= qµ⟨p|γµ|k]. (4.44)

Since this relation holds for an arbitrary qµ, the identity follows. Notice
that the compact notation introduced above allows us to avoid display-
ing the Lorentz indices explicitly.
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• Fierz identity :

[i|γµ|j⟩[k|γµ|l⟩ = 2[ik]⟨lj⟩. (4.45)

Using charge conjugation,

[k|γµ|l⟩ = ⟨l|γµ|k], (4.46)

so that it is enough to prove

[i|γµ|j⟩⟨l|γµ|k] = 2[ik]⟨lj⟩. (4.47)

To this end, consider on the one hand that

[i|γµ/pj/plγµ|k] = [i|γµ|j⟩[jl]⟨l|γµ|k], (4.48)

on the other hand

[i|γµ/pj/plγµ|k] = pj,αpl,β[i|γµγαγβγµ|k]

= 4pj · pl [ik]
= −2[jl]⟨jl⟩[ik]
= 2[jl]⟨lj⟩[ik]. (4.49)

In the second line we used the four-dimensional γ-matrix identity

γµγαγβγµ = 4gαβ 1, (4.50)

which holds in d = 4 spacetime dimensions.

Therefore,
[i|γµ|j⟩[jl]⟨l|γµ|k] = 2[jl]⟨lj⟩[ik], (4.51)

and, after cancelling the common factor [jl], we obtain

[i|γµ|j⟩⟨l|γµ|k] = 2[ik]⟨lj⟩. (4.52)

• Schouten identity :

|i⟩⟨jk⟩+ |j⟩⟨ki⟩+ |k⟩⟨ij⟩ = 0. (4.53)

This identity follows from the simple fact that any three two-component
spinors are linearly dependent. Therefore, given three spinors |i⟩, |j⟩,
and |k⟩, one can write

|k⟩ = a|i⟩+ b|j⟩. (4.54)

Contracting this relation with ⟨i| and ⟨j|, respectively, gives

⟨ik⟩ = b⟨ij⟩, b =
⟨ik⟩
⟨ij⟩

,

⟨jk⟩ = a⟨ji⟩, a =
⟨jk⟩
⟨ji⟩

= −⟨jk⟩
⟨ij⟩

.

(4.55)
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Hence,

|k⟩ = −⟨jk⟩
⟨ij⟩

|i⟩+ ⟨ik⟩
⟨ij⟩

|j⟩. (4.56)

Multiplying by ⟨ij⟩ and using ⟨ik⟩ = −⟨ki⟩, we obtain

|i⟩⟨jk⟩+ |j⟩⟨ki⟩+ |k⟩⟨ij⟩ = 0, (4.57)

which proves the Schouten identity.

Contracting the identity with a fourth spinor ⟨r|, one obtains the more
commonly used form

⟨ri⟩⟨jk⟩+ ⟨rj⟩⟨ki⟩+ ⟨rk⟩⟨ij⟩ = 0. (4.58)

An analogous identity holds for square spinors:

[ri][jk] + [rj][ki] + [rk][ij] = 0. (4.59)

4.1.3 Polarization vectors

For a massless vector boson with momentum k, we introduce an arbitrary
massless reference momentum r, with r ̸= k, and define the polarization
vectors as in [46]

ε+µ (k; r) :=
[k|γµ|r⟩√
2 ⟨kr⟩

, ε−µ (k; r) :=
⟨k|γµ|r]√
2 [kr]

, (4.60)

where the usage of γµ in place of the Pauli matrices is understood.
The arbitrariness in the choice of r reflects gauge invariance: changing the

reference spinor changes the polarization vector by a term proportional to the
momentum kµ, which does not affect gauge-invariant on-shell amplitudes.

The polarization vectors must satisfy some fundamental properties.

• Transversality :

kµε±µ (k; r) = 0, rµε±µ (k; r) = 0. (4.61)

Indeed,

kµε+µ (k; r) =
[k|/k|r⟩√
2 ⟨kr⟩

= 0, rµε+µ (k; r) =
[k|/r|r⟩√
2 ⟨kr⟩

= 0,

kµε−µ (k; r) =
⟨k|/k|r]√
2 [kr]

= 0, rµε−µ (k; r) =
⟨k|/r|r]√
2 [kr]

= 0.

(4.62)

These relations follow from the massless Weyl Eqs. (4.19) for the spinors
associated with k and r.
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• Slashed polarization vectors:

/ε+(k; r) =

√
2

⟨kr⟩
(|k]⟨r|+ |r⟩[k|) , /ε−(k; r) =

√
2

[kr]
(|k⟩[r|+ |r]⟨k|) .

(4.63)
These relations connect the 4-dimensional slashed polarization vectors
with the 2-dimensional spinor variables. Hence, they encode the nota-
tion abuse we have already encountered before.

For example, by inserting /ε+ between two external spinors, one finds

⟨i|/ε+(k; r)|j] = ⟨i|γµ|j] ε+µ (k; r)

=
⟨i|γµ|j] [k|γµ|r⟩√

2 ⟨kr⟩

=

√
2

⟨kr⟩
⟨ir⟩[kj]

= ⟨i|

[ √
2

⟨kr⟩
|r⟩[k|

]
|j]. (4.64)

By exploiting this strategy the slashed polarization vectors are correctly
reproduced.

• Complex conjugation: for real momenta,(
ε+µ (k; r)

)∗
= ε−µ (k; r). (4.65)

Indeed, for real k and r, angle and square spinors are related by complex
conjugation. Therefore,(

ε+µ (k; r)
)∗

=

(
[k|γµ|r⟩√
2 ⟨kr⟩

)∗

=
⟨k|γµ|r]√
2 [kr]

= ε−µ (k; r). (4.66)

• Normalization:
ε+(k; r) · ε−(k; r) = −1. (4.67)

Indeed,

ε+(k; r) · ε−(k; r) = −1

2

[k|γµ|r⟩⟨k|γµ|r]
⟨kr⟩[kr]

= −1

2

2⟨kr⟩[kr]
⟨kr⟩[kr]

= −1. (4.68)

where the Fierz identity was implemented.
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• Same-helicity contractions:

ε+(k; r) · ε+(k; r) = 0, ε−(k; r) · ε−(k; r) = 0. (4.69)

For the positive-helicity case,

ε+(k; r) · ε+(k; r) = −1

2

[k|γµ|r⟩[k|γµ|r⟩
⟨kr⟩2

= − [kk]⟨rr⟩
⟨kr⟩2

= 0. (4.70)

Similarly,

ε−(k; r) · ε−(k; r) = −1

2

⟨k|γµ|r]⟨k|γµ|r]
[kr]2

= −⟨kk⟩[rr]
[kr]2

= 0. (4.71)

• Gauge transformations: changing the reference spinor changes the po-
larization vector by a term proportional to the external momentum kµ.
For the positive-helicity polarization, one finds

ε+µ (k; r̃)− ε+µ (k; r) =
[k|γµ|r̃⟩√
2 ⟨kr̃⟩

− [k|γµ|r⟩√
2 ⟨kr⟩

=
⟨kr⟩[k|γµ|r̃⟩ − ⟨kr̃⟩[k|γµ|r⟩√

2 ⟨kr̃⟩⟨kr⟩

=
[k|γµ (⟨kr⟩|r̃⟩ − ⟨kr̃⟩|r⟩)√

2 ⟨kr̃⟩⟨kr⟩

= − ⟨rr̃⟩√
2 ⟨kr̃⟩⟨kr⟩

[k|γµ|k⟩

= −
√
2

⟨rr̃⟩
⟨kr̃⟩⟨kr⟩

kµ. (4.72)

where in the fourth step we have employed the Schouten identity (4.58),
while in the last step we have used Eq. (4.40). Therefore,

ε+µ (k; r̃) = ε+µ (k; r)+C+(r, r̃) kµ, C+(r, r̃) = −
√
2

⟨rr̃⟩
⟨kr̃⟩⟨kr⟩

. (4.73)

Hence two polarization vectors with different reference spinors differ
only by a gauge transformation. If the amplitude satisfies the Ward
identity [2]

kµM
µ = 0, (4.74)

then the physical quantity ε±µ (k; r)M
µ is independent of the choice of

the reference spinor.
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Remark. For each external vector boson, one is free to choose the corre-
sponding reference spinor ri, with ri ̸= ki. However, this choice must be kept
fixed in all diagrams contributing to the same process. After summing over all
diagrams, the final on-shell amplitude is independent of the reference spinors
ri.

4.1.4 The little group scaling

In this section, we present a powerful tool that can be used together with
the spinor-helicity formalism to infer the form of an on-shell scattering am-
plitude, namely the little group. A somewhat formal discussion of the little
group can be found in Appendix B.2.1. In this section, instead, we provide a
more direct and intuitive approach, starting from the simple case of massless
particles.

The discussion of the spinor helicity formalism in the previous sections,
allowed us to disentangle the presence of left- and right-handed indices be-
longing to the two non-equivalent 2-dimensional irreducible representations
of Lorentz group. This relation was given in Eq. (4.25) as

paȧ = |p⟩a[p|ȧ, p̄ȧa = |p]ȧ⟨p|a. (4.75)

The introduction of little-group techniques follows from noticing that these
relations are invariant under the scaling

|p⟩ → w |p⟩, |p] → w−1|p], (4.76)

which is indeed a little-group transformation, as it leaves the massless mo-
mentum pµ invariant. As reported in Eq. (B.56), the little group of the
momentum pµ does not change the momentum itself, but acts at most on
the internal labels, which we denoted collectively by σ in the Appendix. In
the present massless case, the physically relevant non-trivial part of the little
group is U(1). From a physical point of view, we can straightforwardly jus-
tify this statement. For a massless particle, we can choose a frame in which
pµ = (E, 0, 0, E). The transformations that leave this vector invariant form
the Euclidean group in two dimensions, denoted by E(2). This group con-
tains rotations in the transverse (x, y)-plane, together with two translation-
like generators. The physically relevant finite-dimensional representations
are obtained by requiring the translation-like generators to act trivially on
the states. Therefore, the non-trivial part of the massless little group is its
rotational subgroup,

SO(2) ≃ U(1). (4.77)

In particular, in the spinor representation of a massless momentum, the little-
group transformation is realized as the scaling in Eq. (4.76). For real mo-
menta, w must be a complex phase, so that the reality condition relating
angle and square spinors is preserved. For complex momenta, instead, angle
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and square spinors are independent, and therefore w can be taken to be any
non-zero complex number.

The invariance of an on-shell massless momentum under the U(1) little
group allows one to constrain an on-shell tree-level amplitude without speci-
fying a Lagrangian. In fact, a Feynman amplitude essentially consists of prop-
agators, vertices, and external-line factors. However, the momenta appearing
in propagators and vertices are invariant under little-group transformations.
More explicitly, only the wave functions associated with the incoming and
outgoing particles transform under the little group.

Suppose we write a scattering amplitude involving massless particles en-
tirely in terms of spinor variables. Let i = 1, 2, . . . , n label the external
particles involved, so that we can denote the amplitude as

Mn

(
1h1 , . . . , ihi , . . . , nhn

)
, (4.78)

where we have specified the helicity of each particle and denoted each mo-
mentum pi simply by its label i. Now, the little-group scaling of the external
states is then fixed as follows:

• a scalar external state carries no little-group weight, thus it does not
scale;

• for massless Weyl fermions, the external spinors scale with weight w−2h,
where h = ±1

2 ;

• for massless spin-1 bosons, the polarization vectors have little-group
weight w−2h, with h = ±1. Indeed, under the scaling in Eq. (4.76), the
massless vector bosons in Eq. (4.60) transform as

ε±µ (p; r) −→ w∓2ε±µ (p; r) = w−2hε±µ (p; r), h = ±1. (4.79)

This transformation is the little-group transformation associated with
the external leg of momentum p; the chosen reference spinors are held
fixed. A separate rescaling of the reference spinors would cancel between
the numerator and denominator and leaves the polarization vector hence
unchanged.

Thus, for amplitudes involving only massless particles, little-group covariance
gives a strong constraint. Under the little-group scaling of the spinors as-
sociated with each external particle, the on-shell amplitude must transform
homogeneously with weight −2hi, where hi is the helicity of the i-th particle.
Therefore [47],

Mn

(
1h1 , . . . , ihi , . . . , nhn

)
= w−2hi

i Mn

(
1h1 , . . . , ihi , . . . , nhn

)
(4.80)

This result can be applied to all the nmassless particles involved in the process
of interest.
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4.1.5 Three-point amplitudes from little-group scaling

We now apply the discussion developed so far to the case of three-point
amplitudes. We consider both a top-down and a bottom-up approach. The
former relies on the specification of a Lagrangian, which in this case is the
simple QED Lagrangian. In particular, we use the explicit representation of
the wave functions in terms of spinor variables, Eq. (4.17), together with the
explicit form of the polarization vectors in Eq. (4.60), in order to implement
the spinor-helicity formalism.

Conversely, from a bottom-up perspective, we will eventually recover the
same result, but starting from more general principles. In particular, we will
implement little-group scaling, dimensional analysis, and locality arguments.

Top-down derivation from QED. Consider the three-point QED ampli-
tude involving a massless electron e, a massless positron ē, and a photon γ.
We choose the following helicity configuration and momentum assignments

e−(p1), ē+(p2), γ−(p3),

where all momenta are taken to be incoming. The SM Feynman rule reads [2]

ē+(p2)

e−(p1)

γ−(p3) = ieγµ. (4.81)

Using the QED vertex and the negative-helicity polarization vector, the
amplitude can be obtained in the spinor helicity formalism

M3

(
1−
e− , 2

+
ē+
, 3−γ

)
= ie v̄+(p2)γµu−(p1) ε

µ
−(p3; q)

= ie [2|γµ|1⟩ ⟨3|γµ|q]√
2 [3q]

= ie
1√
2 [3q]

2⟨31⟩[2q]

= −ie
√
2
⟨13⟩[2q]
[3q]

, (4.82)

where in the third line we used the Fierz identity. The result still depends on
the reference spinor q, but this dependence must cancel in the final on-shell
amplitude. Indeed, using momentum conservation, p1 + p2 + p3 = 0 one can
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eliminate q as follows:

⟨13⟩[2q] = ⟨13⟩
⟨12⟩

⟨1|p2|q]

= −⟨13⟩
⟨12⟩

⟨1|(p1 + p3)|q]

= −⟨13⟩
⟨12⟩

⟨1|p3|q]

= −⟨13⟩2

⟨12⟩
[3q]. (4.83)

Substituting this expression into Eq. (4.82), we obtain

M3

(
1−
e− , 2

+
ē+
, 3−γ

)
= ie

√
2
⟨13⟩2

⟨12⟩
. (4.84)

Notice that this final result depends only on angle brackets. This is a
special feature of three-point kinematics with massless external particles. This
fact becomes clear from

⟨12⟩[21] = 2p1 · p2 = (p1 + p2)
2 = p23 = 0. (4.85)

Two important consequences follow:

• Three-point amplitudes depend either on angle brackets or on square
brackets.

Since
⟨12⟩[21] = 0, (4.86)

either ⟨12⟩ = 0 or [21] = 0. The same reasoning applies to the other
pairs of external particles.

Suppose, for instance, that ⟨12⟩ ̸= 0. Then [12] = 0. Moreover, using
momentum conservation,

0 = ⟨1|(/p1 + /p2 + /p3)|3] = ⟨12⟩[23], (4.87)

and therefore
[23] = 0. (4.88)

Similarly, one obtains [13] = 0. Hence, if the angle brackets are non-
vanishing, all square brackets vanish:

[12] = [13] = [23] = 0. (4.89)

Conversely, if the square brackets are non-vanishing, all angle brackets
vanish:

⟨12⟩ = ⟨13⟩ = ⟨23⟩ = 0. (4.90)

Therefore, a non-vanishing three-point amplitude involving only mass-
less particles can depend either on angle brackets or on square brackets,
but not on both.
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• Non-vanishing three-point amplitudes require complex momenta.

For real momenta, angle and square spinors are related by complex
conjugation. Therefore, if all square brackets vanish, the corresponding
angle brackets must vanish as well, and vice versa. This would make
any massless three-point amplitude vanish.

Non-trivial massless three-point amplitudes are therefore naturally de-
fined with complex momenta. In this case, angle and square spinors
become independent variables, and the two kinematic branches are in-
dependent.

Bottom-up derivation from little-group scaling. At this point, we
want to use the spinor-helicity formalism to obtain the tree-level on-shell
three-particle amplitude in a model-independent way, namely without a pri-
ori knowledge of a Lagrangian that dictates the interactions. Suppose that
the amplitude depends only on angle brackets; we will comment on this point
later. The most general three-point ansatz is

M3

(
1h1 , 2h2 , 3h3

)
= c ⟨12⟩x12⟨13⟩x13⟨23⟩x23 , (4.91)

where c is an overall constant. The amplitude scales in the following way:

M3 −→

w
−2h1
1 w−2h2

2 w−2h3
3 M3 (using Eq. (4.80)),

wx12+x13
1 wx12+x23

2 wx13+x23
3 M3 (using Eq. (4.76)).

Equating the two scalings gives
x12 + x13 = −2h1,

x12 + x23 = −2h2,

x13 + x23 = −2h3.

(4.92)

The solution is

x12 = h3 − h1 − h2, x13 = h2 − h3 − h1, x23 = h1 − h2 − h3. (4.93)

Therefore little-group scaling fixes the angle-bracket three-point amplitude to
be

M3

(
1h1 , 2h2 , 3h3

)
= c ⟨12⟩h3−h1−h2⟨13⟩h2−h3−h1⟨23⟩h1−h2−h3 . (4.94)

Applying this formula to

h1 = −1

2
, h2 = +

1

2
, h3 = −1,
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one immediately obtains

M3

(
1−
e− , 2

+
ē+
, 3−γ

)
= c

⟨13⟩2

⟨12⟩
, (4.95)

in agreement with the top-down calculation, with

c = ie
√
2.

We can now comment further on the procedure just described.

• Dimensional analysis provides an additional selection rule.

Let us evaluate the mass dimension of the parameter c appearing in the
amplitude of Eq. (4.94). First, recall that in four spacetime dimensions
an n-point amplitude has mass dimension [47]

[Mn] = 4− n. (4.96)

For a three-point amplitude this gives [M3] = 1. Since each spinor
bracket has mass dimension one, the coupling in the angle-bracket so-
lution has dimension

[c] = 1 + h1 + h2 + h3. (4.97)

For the QED amplitude above this gives [c] = 0, as expected for the
dimensionless electric charge. Other helicity assignments may require a
coupling with non-zero mass dimension; if such a coupling is not present
in the theory, the corresponding amplitude is absent. In particular, if
we set h1 = h2 = h, we must have [c] ̸= 0, which means that

M3

(
1+
e− , 2

+
ē+
, 3±γ

)
= M3

(
1−
e− , 2

−
ē+
, 3±γ

)
= 0. (4.98)

This result is expected from the fact that QED interactions preserve chi-
rality. In the massless limit, this means that the two outgoing fermions
must have equal chirality, namely opposite helicities1.

Let us observe another important point related to the mass dimension
of c. If we set

h1 = +
1

2
, h2 = −1

2
, h3 = +1, (4.99)

and try to use the angle-bracket solution, the coupling would have non-
zero mass dimension, namely [c] = 2. This would seem to suggest
that this amplitude cannot be generated by the dimension-four QED
interaction. However, this cannot be the case. How do we solve this
issue?

1Recall that, in our notation, helicity coincides with chirality for particles, while it is
opposite to chirality for antiparticles.
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Instead of starting from the ansatz in Eq. (4.91), we can consider its
parity conjugate2

M3

(
1h1 , 2h2 , 3h3

)
= c̃ [12]x̃12 [13]x̃13 [23]x̃23 . (4.100)

Following steps analogous to those above, one finds that little-group
scaling fixes the square-bracket exponents in terms of the helicities of
the external particles,

M3

(
1h1 , 2h2 , 3h3

)
= c̃ [12]−h3+h1+h2 [13]−h2+h3+h1 [23]−h1+h2+h3 .

(4.101)
Specializing this equation to the case of the QED vertex, we find the
parity-conjugate QED amplitude

M3

(
1+
e− , 2

−
ē+
, 3+γ

)
= c̃

[13]2

[12]
, (4.102)

with [c̃] = 0, as expected. The remaining non-vanishing helicity configu-
rations can be obtained straightforwardly from Eqs. (4.94) and (4.101).
The configurations with equal fermion and antifermion helicities vanish,
as discussed above.

A natural question arises at this point. If we do not require the overall
coefficient of the amplitude, here denoted by c, to have vanishing mass
dimension, namely if we also allow amplitudes generated by higher-
dimensional operators, how do we know whether the ansatz should be
written in terms of angle brackets or square brackets?

• The role of locality.

To answer the question above, we need to take into account the locality
of the operators that generate a given amplitude. Again, we provide an
example that illustrates the issue. We consider a three-gluon amplitude
with two negative-helicity gluons and one positive-helicity gluon. Using
Eq. (4.94), we find

M3

(
1−g 2

−
g 3

+
g

)
= c

⟨12⟩3

⟨13⟩⟨23⟩
. (4.103)

For brevity, we omit the fully antisymmetric color factor fa1a2a3 , which
ensures Bose symmetry under the exchange of the identical gluons 1 and
2. This amplitude has the correct mass dimension with a dimensionless
coupling c.

2Parity reverses the spatial momentum of a particle. This also flips the sign of the
helicity, which in turn implies that, in order to provide the correct little-group weight, angle
brackets must be exchanged with square brackets and vice versa: ⟨· ·⟩ ↔ [· ·].
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Now, let us try to build the same helicity configuration using the square-
bracket amplitude in Eq. (4.101). This yields

M3

(
1−g 2

−
g 3

+
g

)
= c̃

[13][23]

[12]3
. (4.104)

In this case, the coefficient has non-zero mass dimension, [c̃] = 2.

Therefore, what is the correct physical amplitude between the two?
From Eq. (4.103), we see that the momentum dependence scales as M1,
since spinor brackets carry mass dimension one. This is compatible with
the fact that the amplitude comes from the local cAA∂A interaction
contained in TrFµνF

µν . On the other hand, in Eq. (4.104) the momen-
tum dependence scales as M−1. This means that such an amplitude
would have to come from an interaction term of the form

c̃ AA
∂

□
A.

However, this cannot originate from a local Lagrangian. Therefore, we
discard the amplitude in Eq. (4.104) as unphysical.

By now, the importance of little-group scaling as a tool to determine
model-independent scattering amplitudes should be clear. Moreover, we ob-
served that dimensional analysis provides an additional selection rule for the
determination of an amplitude, together with the requirement that it must
be generated by local operators. These general arguments uniquely fix the
massless three-particle amplitude and can also be used in more complicated
cases that will be explored in the following.

4.2 The massive spinor helicity formalism

Up to this point, we have discussed how to use the spinor helicity formal-
ism to determine tree-level scattering amplitudes. This was done both in a
top-down and a bottom-up approach, applied to three particle scattering pro-
cesses. Now, we wish to extend the formalism to include massive momenta.
This will allow us to consider more complicated scattering processes involving
both massless and massive particles, such as Higgs bosons and quarks.

Some of the techniques discussed in the previous sections for the massless
case can also be directly applied to the massive case. We will point out these
similarities when needed.

A straightforward extension to the massive case can be obtained through
the following argument. Given a massive momentum Pµ, such that P 2 = m2,
and two non-collinear massless momenta qµ and kµ, such that q2 = k2 = 0,
we can write

Pµ ≡ qµ +
m2

2q · k
kµ. (4.105)
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The idea is that, by decomposing a massive momentum as the sum of two
massless momenta, we can reuse many of the tools developed for the massless
spinor-helicity formalism. In particular, from the equation above, we may
write

/P = /q +
m2

⟨kq⟩[qk]
/k. (4.106)

Although this provides a straightforward extension to massive momenta, the
formalism is not particularly efficient. In particular, the covariance of an
amplitude under little-group transformations of the massive momentum is
obscured. To see this, notice that the definition provided in Eq. (4.105) con-
tains three redundant real degrees of freedom. In fact, both massless and
massive momenta possess three real degrees of freedom, given by their four
components subject to the corresponding on-shell condition. These three spu-
rious degrees of freedom are related to the massive little group, which in four
dimensions is SO(3), or equivalently its double cover SU(2) for particles with
spin. Therefore, just as the invariance of a massless momentum /p under the
U(1) little group is manifest in Eq. (4.76), we can make the analogous prop-
erty manifest in the massive case as well.

To this end, it is convenient to introduce a new set of spinors |pI⟩, |pI ]
which carry a manifest SU(2) index I. Explicitly, we can define the momen-
tum spinor variables as

paȧ = |pI⟩a[pI |ȧ, p̄ȧa = |pI ]ȧ⟨pI |a. (4.107)

Therefore, we can also write a massive momentum pµ employing

/p ≡ |pI⟩[pI |+ |pI ]⟨pI |. (4.108)

This momentum is now manifestly invariant under the transformations

|pI⟩ → W I
J |pJ⟩, [pI | →

(
W−1

)J
I [pJ |, (4.109)

where W J
I is a matrix in the SU(2) little group. To raise and lower these in-

dices we can employ the 2-dimensional Levi-Civita tensor defined in Eq. (B.25),
where we simply replace the Lorentz indices with the SU(2) little group ones,
ϵIJ .

Following the conventions of Ref. [46] we write the explicit expressions of
the massive Dirac wavefunctions as

uI(p) =

(
|p⟩Ia
|p]I,ȧ

)
, vI(p) =

(
|p⟩Ia

−|p]I,ȧ
)
,

ūI(p) =
(
−⟨p|aI [p|I,ȧ

)
, v̄I(p) =

(
⟨p|aI [p|I,ȧ

)
.

(4.110)
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Plugging these objects into the momentum Dirac equation (4.11), yields the
massive Weyl equations

paȧ |pI ]ȧ = m |pI⟩a, p̄ȧa |pI⟩a = m |pI ]ȧ,

[pI |ȧ p̄ȧa = −m ⟨pI |a, ⟨pI |a paȧ = −m [pI |ȧ.
(4.111)

For brevity, we collect in Appendix C.1 all the other relevant relations among
massive spinors which we use to set the notation.

4.2.1 hq̄q amplitude from massless to massive

As an intermediate example between the massless and massive spinor he-
licity formalisms, let us consider the Yukawa interaction between the Higgs
boson and a quark–antiquark pair. We take

h(p1), q̄j(p2), qi(p3), with p1 = −p2 − p3, p22 = p23 = m2
q ,

(4.112)
where i, j are colour indices, and the momenta all incoming .

The corresponding Standard Model Feynman rule gives [2]

q̄j(p2)

qi(p3)

h(p1) = −i δij
yq√
2
, (4.113)

where yq =
√
2mq

v is the yukawa coupling of the quark q. In this section,
we first evaluate the squared modulus of the amplitude for this process,∣∣M(h, q̄, q)∣∣2, in the massless case and then extend the calculation to the
massive case using the spinor-helicity formalism. This provides a useful ex-
ample for understanding the connection between the massless and massive
formulations and will also be relevant for the subsequent calculation of Higgs
production in gluon fusion. Finally, as a consistency check, we compare the
resulting amplitude with the one obtained using standard Dirac-spinor tech-
niques.

Massless helicity amplitudes. When the two external fermions are treated
as massless, the only non-vanishing helicity amplitudes are those with equal
helicities, since the Higgs–quark interaction flips chirality:

M
(
1h, 2

+
q̄i , 3

+
qj

)
= −i δij

yq√
2
[32], (4.114)

M
(
1h, 2

−
q̄i , 3

−
qj

)
= −i δij

yq√
2
⟨32⟩, (4.115)

M
(
1h, 2

+
q̄i , 3

−
qj

)
= M

(
1h, 2

−
q̄i , 3

+
qj

)
= 0. (4.116)

These on-shell tree-level amplitudes can be obtained in two equivalent ways:
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• Bottom-up approach. Take Eqs. (4.94) and (4.101), and specialize
them to the present process by setting h1 = 0, h2 = −1

2 and h3 = −1
2 in

the former equation, and h1 = 0, h2 = −1
2 and h3 = −1

2 in the latter3.
Then you just need to match the generic coupling c to the SM one of
Eq. (4.113), obtaining c = −iδij yq√

2
.

• Top-down approach. Start directly from the helicity amplitudes of
the process M

(
1h, 2

±
q̄i , 3

±
qj

)
= −iδij yq√

2
v̄±(p2)u±(p3) and use the explicit

form of the Dirac wave functions in terms of spinor-helicity variables,
namely Eq. (4.17).

This being said, we can easily evaluate the squared amplitude by summing
over all helicities and colors of the particles involved:∣∣M(h, q̄, q)∣∣2

massless
=

∑
hel., col.

|M|2massless

= Nc

y2q
2

([32]⟨23⟩+ ⟨32⟩[23])

= Nc

y2q
2

(2p2 · p3 + 2p2 · p3)

= 2Nc y
2
q p2 · p3. (4.117)

Here, we have implemented Eq. (4.31) to convert the spinor products into
momentum dot products, and also Eq. (4.20) when evaluating the complex
conjugated amplitudes.

Massive amplitude. Let us now turn to the most interesting case, namely
the massive one. As already discussed, in the massive spinor-helicity formal-
ism, helicity is replaced by an SU(2) little-group index. We assign the index
I to leg 3 and the index J to leg 2, and obtain the massive amplitude in a
top-down approach,

MI
J ≡ M

(
1h, 2q̄i,J , 3

I
qj

)
= −i δij

yq√
2
v̄J(p2)u

I(p3)

= i δij
yq√
2

(
⟨3I2J⟩+ [3I2J ]

)
. (4.118)

where the explicit form of the massive Dirac wavefunctions Eq. (4.110) was
used. Clearly, also here a bottom-up approach can be used; however we have
not yet developed the needed tools.

3Notice we are using Eqs. (4.94) and (4.101) as if all particles involved were massless,
though the Higgs boson its clearly not. From a practical point of view this is completely
fine as the Higgs is a scalar, therefore it does not bring about any little group index that
would spoil the equations we are using here.
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Since each external fermion has spin 1/2, each leg carries only one little-
group index, and no symmetrization is required. We will address this point
more accurately later. By exploiting the high-energy limit as prescribed in
Appendix C.2 we correcly reproduce the massless components:

M1
1

mq→0−−−−→ −i δij
yq√
2
[32], M2

2

mq→0−−−−→ −i δij
yq√
2
⟨32⟩, (4.119)

Notice we are taking the massless limit of the kinematic mass, thus we are
keeping the Yukawa coupling constant. We can now proceed to evaluate
the squared modulus of the amplitude by summing over the two little group
indices I, J and color. First, exploiting Eq. (C.3) we obtain(

⟨3I2J⟩
)†

= −[2J3I ],
(
[3I2J ]

)†
= −⟨2J3I⟩. (4.120)

∑
spin, col.

∣∣MI
J

∣∣2 = −Nc

y2q
2

(
⟨3I2J⟩+ [3I2J ]

) (
[2J3I ] + ⟨2J3I⟩

)
= −Nc

y2q
2

[
⟨3I2J⟩[2J3I ] + [3I2J ]⟨2J3I⟩

+ ⟨3I2J⟩⟨2J3I⟩+ [3I2J ][2
J3I ]

]
. (4.121)

Each of the four terms can be evaluated using Eq. (4.107) and the identities
reported in Eq. (C.1). The relevant contractions are

⟨3I2J⟩[2J3I ] = ⟨3I |a
(
|2J⟩a[2J |ȧ

)
|3I ]ȧ

= −⟨3I |a(p2)aȧ|3I ]ȧ

= −(p2)aȧ(p̄3)
ȧa

= −2p2 · p3. (4.122)

[3I2J ]⟨2J3I⟩ = [3I |ȧ
(
|2J ]ȧ⟨2J |a

)
|3I⟩a

= [3I |ȧ(p̄2)ȧa|3I⟩a
= −(p̄2)

ȧa(p3)aȧ

= −2p2 · p3. (4.123)

⟨3I2J⟩⟨2J3I⟩ = ⟨3I |a
(
|2J⟩a⟨2J |b

)
|3I⟩b

= mq ⟨3I |aδba|3I⟩b
= mq ⟨3I |3I⟩
= −mq ⟨3I |3I⟩
= m2

q δ
I
I

= 2m2
q . (4.124)
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[3I2J ][2
J3I ] = [3I |ȧ

(
|2J ]ȧ[2J |ḃ

)
|3I ]ḃ

= −mq [3
I |ȧδȧḃ |3I ]

ḃ

= −mq [3
I |3I ]

= mq [3I |3I ]
= m2

q δ
I
I

= 2m2
q . (4.125)

Therefore, we obtain

∣∣M(h, q̄, q)∣∣2 = Nc

y2q
2

(
4p2 · p3 − 4m2

q

)
= 2Nc y

2
q

(
p2 · p3 −m2

q

)
. (4.126)

As a benchmark for the calculation, we can evaluate the same object using
standard Dirac-spinor techniques, obtaining

∣∣M(h, q̄, q)∣∣2 = ∑
spin, col.

|M|2 = Nc

y2q
2

Tr
[(
/p3 +mq

)(
/p2 −mq

)]
= Nc

y2q
2

(
4p2 · p3 − 4m2

q

)
= 2Nc y

2
q

(
p2 · p3 −m2

q

)
. (4.127)

This equation is exactly the same of Eq. (4.126). Hence, we have managed
to obtain the correct amplitude in case of massive quarks using the massive
spinor helicity formalism.

We conclude that the result in Eq. (4.117) therefore misses the term pro-
portional to m2

q , because the external fermions were treated as massless when
performing the polarization sum.

This example provided a first introduction to massive calculations within
the spinor-helicity framework and made the connection with the massless for-
malism explicit. Moreover, we derived the massive amplitude for this process
using a top-down approach. In the following section, we will instead focus
on the bottom-up construction of massive amplitudes based on little-group
covariance.

4.2.2 Little group scaling in the massive case

As already pointed out, the massive little group in four spacetime dimen-
sions is SU(2). Therefore, massive particles of spin s transform in spin-s
representations of SU(2). In the notation of [48], these representations are
described by the states

|p, sz⟩,
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where

J2|p, sz⟩ = s(s+ 1)|p, sz⟩, J3|p, sz⟩ = sz|p, sz⟩, (4.128)

and J is the total angular momentum operator of the particle. See Ap-
pendix B.2 for further discussion on particle states. Here, s labels the ir-
reducible representation of SU(2), whose dimension is

2s+ 1. (4.129)

Namely, a spin-s representation is spanned by

{|p, s1⟩, . . . , |p, s2s+1⟩} . (4.130)

For our purposes, however, it is more convenient to label the spin-s rep-
resentation by a symmetric rank-2s tensor of SU(2),

ψI1···I2s , (4.131)

where each index Ii = 1, 2 is a little-group index. The generators of SU(2)
act on this object as [48]

(Jaψ)I1···I2s =

(
σa

2

)I1

J1

ψJ1I2···I2s + · · ·+
(
σa

2

)I2s

J2s

ψI1···I2s−1J2s . (4.132)

In this way, the spin-s representation is obtained as the completely symmetric
product of 2s spin-12 representations. This implies that any massive spin rep-
resentation can be built by combining spin-12 representations, and the massive
helicity spinors introduced above are precisely SU(2) doublets.

For instance, an amplitude involving a massive fermion of momentum p1
and a massive spin-2 particle of momentum p2 must carry one little-group
index for the fermion and four symmetrized little-group indices for the other
particle. If particles 3 and 4 are massless with helicities h3 =

3
2 and h4 = −1,

respectively, the amplitude can be written schematically as

M(1I , 2{J1,J2,J3,J4}, 3+
3
2 , 4−1), (4.133)

where the SU(2) little-group indices label massive particles, whereas massless
particles are identified by their helicities. Here, as in the massless case, we
abbreviate the spinor associated with the external leg i as |pi] → |i] or |pi⟩ →
|i⟩.

Under a little-group transformation, this amplitude transforms as

M(1I , 2{J1,J2,J3,J4}, 3+
3
2 , 4−1) −→ (W1)

I
I′ (W2)

J1
J ′
1
(W2)

J2
J ′
2
(W2)

J3
J ′
3
(W2)

J4
J ′
4

× w
−2( 3

2)
3 w

−2(−1)
4 M(1I

′
, 2{J

′
1,J

′
2,J

′
3,J

′
4}, 3+

3
2 , 4−1),

(4.134)



The on-shell way 45

where we employ Eqs. (4.109) and (4.80) for the massive and massless little-
group scalings, respectively. Notice that we use curly brackets to indicate that
the indices J1, J2, J3, J3, J4 must be symmetrized. From this relatively simple
example, we can understand the advantage of employing explicit little-group
indices when defining massive momenta.

More generally, an amplitude with a massive spin-s particle of momentum
pµ1 can be written as [48]

M(1{I1···I2s}, . . .) = |1⟩{I1a1 · · · |1⟩I2s}a2s M{a1,...,a2s}

= |1]ȧ1,{I1 · · · |1]I2s},ȧ2s M̃{ȧ1,...,ȧ2s}

, (4.135)

since, as seen in the previous example, the little-group indices must be man-
ifest for the scaling to work properly. The reduced amplitudes M and M̃ do
not carry any massive little group index and are equivalent, as one can switch
between dotted and undotted spinors by exploiting Eqs. (4.111). Moreover,
they are totally symmetric in the a or ȧ indices; again, this is conventionally
indicated by curly brackets.

Let us now give a “legal” expression for the amplitude in the previous
example, namely an expression with the correct little-group transformation
properties.

Again, consider an amplitude with particles 1 and 2 massive, of spin 1/2
and 2, respectively, and particles 3 and 4 massless, with helicities h3 =

3
2 and

h4 = −1. For the massless particles, little-group covariance fixes the required
weights. Since particle 3 has helicity h3 = 3/2, the amplitude must scale as

M → w−2h3
3 M = w−3

3 M. (4.136)

This implies that the amplitude must contain 3 square spinors of momenum
p3, namely |3]3.

Similarly, since particle 4 has helicity h4 = −1, the amplitude must scale
as

M −→ w−2h4
4 M = w2

4M. (4.137)

Hence, the amplitude must also contain 2 square spinors of momenum p3,
namely |4]2.

For the massive particles, the amplitude must carry the appropriate SU(2)
little-group indices. Therefore, for particle 1 we need one index I, while for
particle 2 we need four symmetrized indices J1, J2, J3, J4.

Two possible legal structures, which reproduce the correct little-group
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weights but do not exhaust all the possibilities, are then

M(1I , 2{J1,J2,J3}, 3+
3
2 , 4−1) = c1 [2

J13] [2J23] [2J33] ⟨4 2J4⟩⟨1I4⟩
+ c2 [2

J13] [2J23] [2J33] ⟨1I2J4⟩⟨4| /p1 /p2|4⟩
+ symmetrization over {J1, J2, J3, J4},

(4.138)
where we require symmetrization over the Ji with i ∈ 1, 2, 3, 4 little group in-
dices. It would clearly be notationally cumbersome to keep all explicit SU(2)
little-group indices in our expressions. Fortunately, this is not necessary. We
will denote massive spinor-helicity variables in boldface and suppress their
SU(2) little-group indices. Since these indices are always completely sym-
metrized, they can be restored unambiguously whenever needed. With this
convention, expressions such as the one above can be written in the compact
form

M(1s=
1
2 ,2s=2, 3+

3
2 , 4−1) = [23]3

(
c1 ⟨42⟩⟨14⟩+ c2 ⟨12⟩⟨4| /p1 /p2|4⟩

)
. (4.139)

This expression would otherwise be written as

[2{J1,J2,J3 3]3
(
c1 ⟨4 2J1,J2,J3}⟩⟨1{I4⟩+ c2 ⟨1I} 2J1,J2,J3}⟩⟨4| /p1 /p2|4⟩

)
. (4.140)

It is important to stress that, for massive particles, there is no analogue
of the usual massless helicity weight. Therefore, expressions involving mas-
sive spinors may look, from a purely massless point of view, as if they were
combining terms with different helicity weights. This is not a problem. The
massive spinors transform as SU(2) little-group tensors, and the suppressed
little-group indices ensure that the full expression has the correct transforma-
tion properties.



Chapter 5

Amplitude method at tree level

What we aim to do in this thesis is to extend the “amplitude method” to
the one-loop level, in the case of Higgs production via gluon fusion. In this
section, we review what we exactly mean by “amplitude method”, looking
at tree-level examples. Understanding the working mechanism at tree level
is indeed necessary for its later extension to one loop. Moreover, the former
case is well established in the literature, for instance, in Refs. [49–51].

As presented in Sec. 4.1.5, little-group scaling efficiently constrains mass-
less tree-level amplitudes, together with dimensional analysis and the locality
of the operators. In this section, we want to focus on this subject and extend
the discussion to the massive case. To this end, we will explicitly imple-
ment the massive little-group scaling presented in Sec. 4.2.2, for which no
examples were given. Although not explicitly implemented in this thesis, we
will also give some hints on how to treat higher-point tree-level amplitudes.
Special care must be taken when treating these amplitudes. The point is
that their form is determined not only by the general principles stated above,
giving the so-called “bootstrapped” part, but also by a “factorizable” part,
which comes from gluing together the lower-point on-shell amplitudes they
are made of. Mastering these two methods makes it possible to derive on-shell
scattering amplitudes from a bottom-up perspective, without relying on prior
knowledge of a Lagrangian. In this sense, we usually call these amplitudes
model-independent. What we have just discussed is exactly what we mean
by the “amplitude method”.

The program of this section is therefore to first present a general discussion
on the topic and then compute some scattering amplitudes of interest at tree
level. The first is the hgg process, for which we provide a matching onto
SMEFT. Thereafter, we will apply the amplitude method to the processes
htt̄ and t̄tg. These are of fundamental importance for the extension of the
amplitude method to one loop in the hgg process.

47
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Finally, we stress that we will not explicitly compute amplitudes which re-
quire a factorizable part. To see how factorizable contributions are evaluated
in higher-point amplitudes, see for instance Refs. [2, 46,49,50].

5.1 Bootstrapping and gluing on-shell am-
plitudes

As briefly reviewed in Sec. 3, effective field theories provide a systematic
description of possible new physics arising at high energy and parametrized
through an expansion in inverse powers of a heavy scale Λ. In the conven-
tional Lagrangian approach, this requires the construction of a complete set of
independent local operators, followed by the derivation of the corresponding
Feynman rules, similarly to what was described for SMEFT in Sec. 3.2. What
we do here is to change this perspective. Since the quantities that ultimately
enter physical observables are on-shell scattering amplitudes, it is more nat-
ural to formulate the EFT expansion directly at the level of amplitudes.

An on-shell amplitude is constrained by Lorentz invariance, little-group
covariance and locality. unitarity and the statistics of identical particles.
These principles can be used to determine the allowed kinematic structures
without referring explicitly to a Lagrangian or to a particular choice of opera-
tor basis. In this formulation, redundancies associated with field redefinitions
are absent from the outset, since they do not affect the physical S-matrix.

A general n-point on-shell amplitude may be written schematically as

Mn = T
∑
α

cα
(
{sij}

)
⟨. . .⟩Aα [. . .]Bα , (5.1)

where T denotes an invariant tensor carrying the internal quantum numbers of
the external states, e.g. color, whereas ⟨. . .⟩ and [. . .] represent contracted he-
licity spinor structures. Their exponents are fixed by the little-group weights
of the external states, both for massless and massive particles. The coefficients
cα are Lorentz-invariant functions of the generalized Mandelstam variables

sij = (pi + pj)
2, (5.2)

or, more generally, of independent multiparticle invariants. Throughout this
discussion, all external momenta are taken to be incoming. Eq. (5.1) is what
we mean by the bootstrapping of an amplitude. We have already seen that
the main ingredient we use here is little-group scaling, as shown in Eqs. (4.80)
and (4.135), for the massless and massive cases, respectively.

Let us now focus on the so-called factorizable part of the amplitude. At
tree level, locality implies that the only singularities of the amplitude are sim-
ple poles associated with physical internal propagators. Notice that this point
is one of the most evident differences between tree-level and loop-level am-
plitudes, since in the latter a much more complicated non-analytic structure
emerges from the integrations over the loop momenta. Sticking to tree-level
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amplitudes, consider a channel with momentum Pi; the residue at the pole
P 2
i = m2

i must factorize into a product of lower-point on-shell amplitudes,

Res
P 2
i =m2

i

Mn =
∑
σi

ML

(
. . . , iσi

)
MR

(̃
i−σi , . . .

)
, (5.3)

where the sum runs over the physical polarization or little-group states of the
exchanged particle. Clearly, the state ĩ carries momentum opposite to that
of i.

It is therefore useful to decompose the full tree-level amplitude as

Mn = MF
n +MNF

n , (5.4)

whereMF
n is the factorizable contribution containing all physical poles, whereas

MNF
n is a local, non-factorizable contribution with no poles. Obtaining both

parts is what we mean by the “amplitude method”.
The two parts are constructed in different but complementary ways. The

factorizable part is obtained by gluing lower-point amplitudes across all al-
lowed physical channels, while the non-factorizable part is obtained by boot-
strapping all local spinor structures compatible with the quantum numbers
and symmetries of the process, as shown in Eq. (5.1).

For example, the factorizable contribution to a four-point amplitude can
be constructed as

MF
4 (ψ1, ψ2, ψ3, ψ4) = −

∑
channels

∑
σV

M3(ψi, ψj , ψ
σV
V )M3(ψk, ψℓ, ψ̃

σV
V )

sij −m2
V

, (5.5)

where i, j, k, ℓ ∈ {1, 2, 3, 4}, ψV is the particle of mass mV being exchanged,
and σV labels its little-group states. The first sum runs over all possible
factorization channels, while the second implements the contraction over the
little-group indices of the internal particle. Here, ψ̃V denotes the same parti-
cle as ψV , but with opposite helicity and momentum, since each three-point
amplitude requires all particles to be incoming. This prescription allows the
full amplitude to reproduce the correct poles and residues. For higher-point
amplitudes, the same principle can be applied recursively, although additional
care is needed to organize the different factorization channels and avoid over-
counting.

The remaining contribution,MNF
n , contains the information that cannot be

reconstructed from lower-point amplitudes. Since all singularities are already
contained in MF

n, its coefficients are analytic functions of the independent
Mandelstam invariants. They can therefore be expanded as

cα
(
{sij}

)
= c(0)α +

1

Λ2

∑
i<j

c
(1)
α,ijsij

+
1

Λ4

∑
i<j
k<ℓ

c
(2)
α,ij;kℓsijskℓ + · · · ,

(5.6)
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where the powers of 1/Λ displayed explicitly account only for the additional
suppression associated with increasing powers of the Mandelstam invariants.
Depending on the spinor-helicity structure labelled by α, the leading coeffi-

cient c
(0)
α may itself start at order 1/Λn, with n fixed by dimensional anal-

ysis. This expansion naturally organizes the amplitude according to its en-
ergy growth. Terms containing higher powers of the Mandelstam invariants
correspond to interactions of increasing canonical dimension and must be ac-
companied by increasing powers of the EFT suppression scale. At this stage,
Bose symmetry can also be imposed: if identical particles are present among
the external states, invariance of the amplitude under their exchange relates
some of the coefficients appearing in the expansion. When matched to a La-
grangian description, the independent coefficients appearing in the on-shell
amplitude are related to linear combinations of Wilson coefficients.

As a final comment, notice that gauge redundancy does not enter explicitly
in this construction because the amplitudes are written directly in terms of
physical on-shell states. For external massless gauge bosons, the combination
of little-group covariance, locality and consistent factorization ensures that
the final result possesses the correct gauge-invariant physical content. In this
sense, gauge invariance is implemented directly at the level of the observable
amplitude.

In the following, the “amplitude method” is illustrated through explicit
examples.

5.1.1 Bootstrapping hgg

Let us consider the three-point amplitude involving one massive scalar and
two massless gluons. The most general ansatz built out of square brackets is

M
(
h, 1a,h1

g , 2b,h2
g

)
= δab[12]nc−d(s12,Λ), (5.7)

where a and b are color indices and c−d is an analytic function of the gen-
eralized Mandelstam variables, which in this case reduce to the Higgs mass
squared,

s12 = (p1 + p2)
2 = m2

h, (5.8)

and of Λ, which parametrizes the scale of an unknown high-energy theory.
The mass dimension of c−d is

[c−d] = −d = 1− n. (5.9)

Under little-group transformations, the amplitude scales in two equivalent
ways:

M3 −→

{
t−2h1
1 t−2h2

2 M3 (using Eq. (4.80)),

t−n
1 t−n

2 M3 (using Eq. (4.76)).
(5.10)
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Notice that the scalar particle does not contribute any little-group weight.
Comparing the two scaling behaviours gives

n = 2h1 = 2h2, (5.11)

and therefore
h1 = h2. (5.12)

Thus, the amplitude vanishes for opposite-helicity gluons, while for h1 =
h2 = +1 one finds n = 2. This has a straightforward physical interpretation
in terms of total angular momentum conservation in a scattering process. For
convenience, consider a Higgs boson at rest and picture its decay into two
gluons in the center-of-mass frame. Since the Higgs boson is a spin-0 particle,
the total angular momentum of the final state must also vanish. This can
be achieved if the spins of the two gluons, which are emitted with opposite
three-momenta due to momentum conservation, either both point along their
respective momentum directions or both point opposite to them. In other
words, the only possible helicity configurations are precisely those predicted
by the spinor-helicity formalism.

The positive-helicity amplitude is therefore

M
(
h, 1a,+g , 2b,+g

)
= δab[12]2c−1(s12,Λ). (5.13)

Here, since the coefficient c of the amplitude has mass dimension of −1, we
can write

c(m2
h,Λ) =

1

Λ
c̃

(
m2

h

Λ2

)
, (5.14)

where c̃ is dimensionless. Locality implies that c̃ is analytic and can be ex-
panded as

c̃

(
m2

h

Λ2

)
=

∞∑
n=0

cn

(
m2

h

Λ2

)n

. (5.15)

Absorbing this expansion into the effective coefficient c++
hgg, the most general

three-point amplitude becomes

M
(
h, 1a,+g , 2b,+g

)
= δab

c++
hgg

Λ
[12]2. (5.16)

Notice that, with respect to the discussion in Sec. 4.1.5, here we allow for a
non-zero mass dimension of the coefficient c. This hints at the presence of a
higher-dimensional operator, specifically one of dimension 6, which generates
this amplitude in the first place. Before looking at the connection between the
amplitude and the EFT operators from which it may be generated, let us first
comment on the other non-vanishing helicity configuration of the amplitude.

As already pointed out in the general discussion of three-point on-shell
amplitudes in Sec. 4.1.5, the negative-helicity configuration requires a different
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ansatz from the one in Eq. (5.7), namely one built out of angle brackets. If
we used the square bracket ansatz instead, a manifestly non-local amplitude
would be generated and should therefore be discarded.

In particular, for the negative-helicity configuration, we should instead
start from

M
(
h, 1a,−g , 2b,−g

)
= δab⟨12⟩nc̃−d(s12,Λ). (5.17)

In this case, following steps similar to those above, we readily obtain

M
(
h, 1a,−g , 2b,−g

)
= δab

c−−
hgg

Λ
⟨12⟩2. (5.18)

As expected, this amplitude is the parity conjugate of the positive-helicity
configuration. This is, again, a confirmation of the correct implementation
of the spinor-helicity formalism. Notice that the coefficient c++

hgg can be in

general different from c−−
hgg. On considering a purely CP-even theory, the two

coefficients must be equal to each other. This is for example the case of the
SM in which

∣∣∣MSM
(
h, 1a,+g , 2b,+g

)∣∣∣2 = ∣∣∣MSM
(
h, 1a,−g , 2b,−g

)∣∣∣2 . (5.19)

Matching onto SMEFT. We now consider for simplicity the amplitude
with all positive helicity configuration. We saw that the emergence on the
inverse of the EFT scale Λ must hint to the presence of dimension-6 operators.
In this context, SMEFT provides this kind of contribution through a subset
of operators we already pointed out in Sec. 3.2 which are

QφG =
(
φ†φ

)
GA

µνG
Aµν , Q

φG̃
=
(
φ†φ

)
GA

µνG̃
Aµν . (5.20)

The relevant Feynman rule that can be obtained from these operators is re-
ported in Eq. (A.17). These two operators are CP-even and CP-odd, respec-
tively.

Now, we can match the SMEFT Wilson coefficients CφG and C
φG̃

onto

the c++
hgg coefficient appearing in the bootstrapped amplitude. We can do this

analytically in two steps; first evaluate the SMEFT amplitude in the spinor
helicity formalism, then confront what we obtained with Eq. (5.16). Notice
we must declare the helicities of the gluons from the outset.
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M
(
h, 1a,+g , 2b,+g

)
SMEFT

=

ga,+µ (p1)

gb,+ν (p2)

h(p)

=
4iv

Λ2
δab
[
CφG (−p1 · p2 gµν + pν1p

µ
2 ) + C

φG̃
ϵµνρσp1ρp2σ

]
ϵ+µ (p1) ϵ

+
ν (p2)

=
1

Λ2

[
4iv δabCφG

(
−
m2

h

2

)
[12]2

m2
h

+ 2v δabC
φG̃

[12]2

]

=
δab[12]2

Λ2

(
−2iv CφG + 2v C

φG̃

)
= −2iv

Λ2
δab[12]2

(
CφG + iC

φG̃

)
.

(5.21)
where we used the following relations

• p1 · p2 =
m2

h
2 from the kinematics of the process;

• ϵ+(p1; p2) · ϵ+(p2; p1) = [12]2

m2
h
. Using the definition of the polarization

vectors in Eq. (4.60), and choosing the reference momenta as r1 = p2
and r2 = p1, we obtain

ε+(p1; p2) · ε+(p2; p1) =
1

2

[1|γµ|2⟩[2|γµ|1⟩
⟨21⟩⟨12⟩

=
[12]���⟨12⟩
⟨21⟩���⟨12⟩

=
[12]2

⟨21⟩[12]

=
[12]2

m2
h

, (5.22)

where Eqs. (4.45) and (4.31) were used.

• p1ρp2σε
+
µ (p1)ε

+
ν (p2)ϵ

µνρσ = − i
2 [12]

2. A proof is provided in Appendix B.1.1.

The result in Eq. (5.22) can be now matched onto the general on-shell
parametrization derived above in Eq. (5.16). Comparing this expression with
the SMEFT amplitude, we obtain the matching relation

c++
hgg = −2iv

Λ

(
CφG + iC

φG̃

)
. (5.23)
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This result makes explicit how the dimension-five on-shell interaction is gen-
erated, within the SMEFT, by dimension-six gauge-invariant operators after
electroweak symmetry breaking. In particular, the factor v/Λ originates from
the insertion of the Higgs vacuum expectation value in QφG and Q

φG̃
. For a

matching onto SMEFT up to order 1/Λ2 see also Ref. [49].
By following a similar calculation, one finds that the matching of the all

negative-helicity amplitude onto SMEFT yields

c−−
hgg = −2iv

Λ

(
CφG − iC

φG̃

)
, (5.24)

which differs from c++
hgg by a sign difference on C

φG̃
. This is expected from

the fact that in a CP-even theory c++
hgg = c−−

hgg, which implies at the level of
SMEFT that C

φG̃
= 0.

5.1.2 Bootstrapping htt̄

We now consider the three-point htt̄ amplitude, which will serve as one
of the building blocks for the gluon-fusion Higgs-production amplitude dis-
cussed in Ch. 7. Here, we derive its general on-shell form. As for the hgg
amplitude, htt̄ does not have a factorizable part, being a three-particle am-
plitude. Therefore, all we need to do is bootstrap its non-factorizable part.
To this end, we exploit Eq. (4.135), which constrains the amplitude to be of
the following form

M(1h,2ti ,3t̄j ) = δij
(
cLLhtt̄⟨32⟩+ cRR

htt̄ [32]
)
. (5.25)

Here, we are implementing the bold notation to avoid showing explicitly the
little-group indices of t and t̄. It is natural to ask whether a structure of the
form

⟨3|/p1|2] (5.26)

should also be considered, as /p1 is invariant under little-group transforma-
tions. We can recast this term in the following form

⟨3|/p1|2] = ⟨3K |(−/p2 − /p3)|2
J ]

= −⟨3K |/p2|2
J ]− ⟨3K |/p3|2

J ]

= −mt⟨32⟩+mt[32]. (5.27)

Here, mt is the top-quark mass, and we have exploited momentum conser-
vation, Eqs. (4.26), and the massive Weyl equations (4.111). Hence, the
independent bootstrapped structures contained in Eq. (5.25) already account
for a term such as ⟨3|/p1|2].

What is different with respect to the SM amplitude? In Sec. 4.2.1, we
already encountered the amplitude involving a Higgs and two quarks. There,
we made use of a top-down approach, starting from the SM interaction vertex.
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We report here the result obtained in Eq. (4.118), adapting the momentum
definitions:

M(1h,2ti ,3t̄j ) = −i δij
yt√
2
(⟨32⟩+ [32]) . (5.28)

We straightforwardly notice that matching to the SM provides the following
values for the coefficients cLLhtt̄ and c

RR
htt̄ of the bootstrapped amplitude:

SM : cLLhtt̄ = cRR
htt̄ = −i yt√

2
. (5.29)

The fact that in the SM the two coefficients are equal to each other reflects
the parity conservation of the interaction. The SM operator ht̄t is indeed
parity conserving; therefore, applying a parity transformation to Eq. (5.28),
thus exchanging angle and square brackets, leaves the amplitude unchanged.
Conversely, the model-independent expression for the amplitude allows for a
more general interaction in which parity can also be violated, for instance via
an operator of the form iht̄γ5t. This can be seen more explicitly by recasting
Eq. (5.25) as

M(1h,2ti ,3t̄j ) = δij

[
cRR
htt̄ + cLLhtt̄

2
(⟨32⟩+ [32]) +

cRR
htt̄ − cLLhtt̄

2
(−⟨32⟩+ [32])

]
.

(5.30)
The second term on the right-hand side is precisely the parity-violating term,
which changes sign under a parity transformation. Also, as expected, if the
two coefficients cLLhtt̄ and c

RR
htt̄ are equal, as in the SM, the parity-violating term

vanishes.
Let us now comment on the choice of notation for the coefficients of the

amplitude, which coincides with that of [46]. In cRR
htt̄ and cLLhtt̄ , the RR and

LL chirality pairs give rise to chirality-violating terms, which is consistent
with the fact that the Higgs boson flips chirality in this interaction. We stick
to this notation since it makes the chiral structure of the spinors manifest.
More explicitly, ⟨32⟩ and [32] are Lorentz-invariant contractions of spinors
transforming in the left- and right-handed Weyl representations, respectively.
Although their Lorentz indices are fully contracted, they retain the suppressed
SU(2) little-group indices associated with the two massive external particles.

As a final remark, we highlight the fact that the amplitude of Eq. (5.25)
can be matched onto its SMEFT counterpart, whose Feynman rule is reported
in Eq. (A.18). From a qualitative comparison, we can see that the combina-
tion (cRR

htt̄ + cLLhtt̄)/2 should account for a simple modification of the Yukawa
coupling due to the presence of the real part of the Wilson coefficient C33

uφ,

whereas the parity-violating coefficient (cRR
htt̄ − cLLhtt̄)/2 can be matched onto

the imaginary part of the same Wilson coefficient. We will not make the
matching explicit here, as it will be performed in Ch. 7 when matching the
one-loop Higgs production via gluon-fusion process. Here, we only wanted to
make a qualitative connection with SMEFT.
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5.1.3 Bootstrapping t̄tg

The last on-shell amplitude we want to determine via bootstrapping is
the interaction between a gluon and a pair of top and anti-top quarks. This
amplitude will be of fundamental importance when studying the one-loop
production of a Higgs via gluon fusion. We start from the positive-helicity
configuration,

M
(
1t̄i ,2tj , 3

a,+
g

)
, (5.31)

As before, we use the bold notation to keep the massive little-group indices
implicit. Since particles 1 and 2 are massive spin-1/2 states, each of them car-
ries one SU(2) little-group index. To bootstrap this amplitude, we implement
the square-spinor representation of Eq. (4.135); the amplitude can therefore
be written as

M
(
1t̄,2t, 3

+
g

)
= |1]ȧ|2]ḃMȧḃ, (5.32)

where all the dependence on the massless particle is contained in Mȧḃ. More-
over, we are omitting the color factor (T a)ji that will be restored at the end
of the derivation.

The reduced amplitude Mȧḃ is strongly constrained by the massless little
group, which dictates the scaling of the square and angle spinors as reported
in Eq. (4.76). In particular, under

|3⟩ −→ w3|3⟩, |3] −→ w−1
3 |3], (5.33)

an amplitude containing a particle of helicity h3 must transform as

M −→ w−2h3
3 M. (5.34)

We say that particle 3 carries helicity weight h3. For a positive-helicity gluon,
h3 = +1, and therefore

M
(
1t̄,2t, 3

+
g

)
−→ w−2

3 M
(
1t̄,2t, 3

+
g

)
. (5.35)

Since the massive spinors |1] and |2] are unaffected by the massless little-
group transformation of particle 3, the entire weight w−2

3 must be carried by
Mȧḃ.

A first possibility is immediate. The tensor

Mȧḃ = [3|ȧ[3|ḃ (5.36)

has precisely the required weight, since each |3] transforms as w−1
3 . It therefore

generates the legal structure

M
(
1t̄,2t, 3

+
g

)
⊃ [31][32]. (5.37)

However, this is not the only possible structure. In two-component spinor
space, a rank-two dotted tensor can also contain an antisymmetric part pro-
portional to ϵȧḃ. Since ϵȧḃ itself carries no little-group weight, it has to be
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multiplied by a scalar quantity transforming as w−2
3 . Such a quantity natu-

rally arises from the special kinematics of the three-point amplitude.
To see this, consider the following two objects

|3⟩, /p1|3]. (5.38)

Their spinor contraction vanishes:

⟨3|/p1|3] = pµ1 ⟨3|γµ|3]
= 2p1 · p3
= (p1 + p3)

2 − p21 − p23

= (−p2)2 −m2
t

= 0. (5.39)

Here we have used momentum conservation assuming all particles to be in-
coming and on shell,

p1 + p2 + p3 = 0, p21 = p22 = m2
t , p23 = 0. (5.40)

The above condition implies that |3⟩ and /p1|3] are not independent. We can
therefore define a scalar quantity x through

/p1|3] = x |3⟩. (5.41)

The proportionality coefficient can be extracted by introducing an arbitrary
auxiliary spinor |r⟩. Contracting the previous relation with ⟨r| gives

x =
⟨r|/p1|3]
⟨r3⟩

. (5.42)

Under the little-group transformation, we have

x −→ w−2
3 x, (5.43)

since the numerator contains one |3] and therefore scales as w−1
3 , whereas the

denominator contains one |3⟩ and scales as w3. Thus, x carries exactly the
helicity weight required for a positive-helicity gluon. We can consequently
construct the second possible tensor structure as

Mȧḃ =
⟨r|/p1|3]
⟨r3⟩

ϵȧḃ, (5.44)

which gives

M
(
1t̄,2t, 3

+
g

)
⊃ [12]

⟨r|/p1|3]
⟨r3⟩

, (5.45)
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Therefore, up to scalar coefficients, the positive-helicity amplitude contains
two independent structures,

[13][23], [12]
⟨r|/p1|3]
⟨r3⟩

. (5.46)

Before putting together these two structures, we can work further on the
latter. One can make use of the following identity

[12]
⟨r|/p1|3]
⟨r3⟩

= mt
⟨r1⟩[32] + ⟨r2⟩[31]

⟨r3⟩
+ [13][23]. (5.47)

whose derivation is reported in Appendix C.4. Making use of the positive-
helicity slashed polarization vectors defined in Eq. (4.63), the previous relation
reads

[12]
⟨r|/p1|3]
⟨r⟩

=
mt√
2

(
⟨1|/ε+3 |2] + ⟨2|/ε+3 |1]

)
+ [13][23], (5.48)

Hence, instead of using [12]x and [13][23] as a basis, we may equivalently
choose the polarization-dependent structure and the pure square-bracket struc-
ture. The general positive-helicity amplitude can then be parametrized as

M
(
1t̄i ,2tj , 3

a,+
g

)
= (T a)ji

(
cgt̄t

(
⟨1|/ε+3 |2] + ⟨2|/ε+3 |1]

)
+ cRRR

gt̄t [13][23]
)
.

(5.49)
Here, we have also restored the color structure with (T a)ji.

The negative-helicity amplitude follows from an entirely analogous argu-
ment. In this case the required massless little-group weight is w+2

3 , and the
roles of angle and square spinors are exchanged. One can define the corre-
sponding quantity

x̃ =
[r|/p1|3⟩
[r3]

, x̃ −→ w+2
3 x̃, (5.50)

and construct the two independent structures

⟨13⟩⟨23⟩, ⟨12⟩ x̃. (5.51)

Equivalently, choosing again a basis involving the polarization vector, the
negative-helicity amplitude can be written as

M
(
1t̄i ,2tj , 3

a,−
g

)
= (T a)ji

(
cgt̄t

(
⟨1|/ε−3 |2] + ⟨2|/ε−3 |1]

)
+ cLLLgt̄t ⟨13⟩⟨23⟩

)
.

(5.52)
Let us further analyze the amplitudes we obtained. Using dimensional anal-
ysis, the couplings cRRR

gt̄t and cLLLgt̄t have mass dimension −1, which hints at
the presence of a dimension-6 operator generating these couplings, hence a
BSM interaction. Indeed, as can be inferred from the SMEFT Feynman rule
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reported in Eq. (A.19), an additional structure with respect to the SM is gen-
erated by the so-called chromomagnetic operator. Conversely, the coefficient
cgt̄t is dimensionless, hinting that the operator that generates it is the renor-
malizable QCD interaction vertex.

What we do now, instead, is match the bootstrapped amplitude onto the
SM one. This will be important in order to benchmark the future computation
of hgg at one loop. We can do this using the explicit expressions for the Dirac
wavefunctions in the massive formalism given in Eq. (4.110):

ga,+(p3)

t̄ Jj (p1)

t Ii (p2)

= −igs (T a)ji ūI(2)γµv
J(1) εµ+(p3, r)

= −igs (T a)ji
(
−⟨2|αI [2|I,α̇

)( 0 (σµ)αβ̇
(σ̄µ)α̇β 0

)( |1⟩Jβ
−|1]J,β̇

)
εµ+(p3, r)

= −igs (T a)ji
(
⟨2|/ε+3 |1] + ⟨1|/ε+3 |2]

)
. (5.53)

In the calculation, we assigned the SU(2) little-group indices I and J to par-
ticles 2 and 3, respectively. The matching between Eq. (5.52) and Eq. (5.53)
then reads

SM : cgt̄t = −igs, cRRR
gt̄t = 0. (5.54)

The fact that cRRR
gt̄t = 0 in the SM confirms our predictions. In the case of

negative-helicity gluons, we clearly obtain

SM : cLLLgt̄t = 0. (5.55)





Chapter 6

One-loop amplitudes and gen-
eralized unitarity

It is now time to go beyond tree level and consider one-loop amplitudes.
In this section, we aim to review some of the main results concerning one-
loop amplitudes, such as the possibility of expressing them in terms of a
basis of only four types of scalar integrals. This result is of fundamental
importance for introducing generalized unitarity methods, which in fact aim
at determining the coefficients of this expansion, thus effectively evaluating
the one-loop amplitude.

Before doing so, we will first briefly focus on the so-called Passarino–
Veltman (PV) reduction, which is a powerful tool that allows tensor integrals
to be reduced to scalar integrals, since the former are the ones that usually
emerge from one-loop diagram computations. We then proceed by reviewing
the cutting rules, making contact with the well-known optical theorem. This
is done in order to introduce the generalized unitarity method in a natural
way.

To systematize the use of this method, it is convenient to introduce the van
Neerven–Vermaseren parametrization of the loop momentum. We present it
for a generic N -point amplitude in D dimensions in order to be as general as
possible. A particularly useful feature of the van Neerven–Vermaseren basis is
that it provides a natural bridge between integrand reduction and generalized
D-dimensional unitarity.

6.1 Basic properties of one-loop integrals

In general, when going from tree level to loop level, the main difference
is the emergence of the so-called Feynman integrals. These are integrals over
the loop momenta of a given diagram and require specific techniques in order

61
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to be evaluated. Here, we do not provide an exhaustive discussion of the
subject, but only introduce the theoretical tools needed for this thesis.

Given an N -point one-loop amplitude, the following type of integral nat-
urally emerges in the computation:

IN ∼
∫

dDl

(2π)D
N(l)[

(l + q0)2 −m2
1

][
(l + q1)2 −m2

2

]
· · ·
[
(l + qN−1)2 −m2

N

] ,
(6.1)

where the momenta qj are obtained from the external momenta pj as follows

qj =

j∑
k=1

pk, q0 = 0, with
N∑
k=1

pk = 0, (6.2)

and N(l) is a polynomial in the loop momentum l and in the external kine-
matic variables. Throughout, the Feynman +iϵ prescription is understood in
all propagator denominators and will be suppressed unless explicitly needed.
Fig. 6.1 provides the diagrammatic representation of this loop integral. We
define a scalar integral as the special case in which N(l) = 1. The general
goal is to compute IN efficiently.

p1

p2

p3
p4

pN−1

pN

l

l + q1

l + q2 l + q3

l + qN−1

m1

m2

m3 m4

mN

...

Figure 6.1: Generic one-loop N -point diagram. All external momenta are taken to
be incoming, with qj =

∑j
k=1 pk.

An important feature of one-loop integrals is that Feynman integrals may
be UV divergent. In particular, if the polynomial N(l) contains a sufficiently
high power of the loop momentum, the Feynman integral may diverge in
the ultraviolet (UV) region. From simple power counting, we can observe
that IN is UV divergent if it contains tensor integrals of rank r with r ≥
2N − 4. This follows from the fact that each propagator in the denominator
of IN contributes two powers of the loop momentum l. This immediately
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implies that only one-point and two-point scalar integrals are UV divergent.
Moreover, the highest rank of an N -point one-loop diagram is r = N in
renormalizable theories such as the SM [15]. This implies that only one-,
two-, three-, and four-point one-loop integrals can be UV divergent, whereas
five- and higher-point one-loop integrals are necessarily ultraviolet finite.

An important point concerning loop amplitudes is how to deal with the
resulting divergences. Loop integrals require the so-called regularization and
renormalization procedures in order to obtain a completely finite result for
a given process of interest. There exist different kinds of regularization for
divergent diagrams and different renormalization schemes. We refer to stan-
dard textbooks for a detailed discussion of these subjects [1, 2]. Commonly,
one employs dimensional regularization, as it provides an economical tool to
deal with divergences in loop integrals. In this case, the dimensionality of
spacetime is set to D = 4−2ϵ, with ϵ a small positive parameter. In this way,
UV divergences arise as poles in the variable ϵ and can therefore be removed
in a straightforward way once a renormalization scheme has been defined.

Up to the required order in ϵ, a generic one-loop integral with four-
dimensional external kinematics can be reduced to a linear combination of
scalar one-, two-, three-, and four-point integrals, together with a rational
contribution [15],

IN =
∑
j

c4,jD
(j)
0 +

∑
j

c3,jC
(j)
0 +

∑
j

c2,jB
(j)
0 +

∑
j

c1,jA
(j)
0 +R+O(D−4). (6.3)

Here, the coefficients cn,j contain the process-dependent kinematic infor-
mation and are evaluated in D = 4, namely, they do not depend on ϵ. More-
over, R denotes the rational part whose contribution originates from informa-
tion that is lost if the loop momentum and numerator algebra are restricted to
four dimensions. For instance explicitD-dependence in tensor or spin algebra,
generates dimension-shifted integrals and O(ϵ) coefficients. When combined
with ultraviolet or infrared poles, these terms can leave finite rational re-
mainders. The integrals appearing in the expansion, D0, C0, B0, A0, carry a
subscript 0, indicating that they are scalar integrals. They are called box, tri-
angle, bubble, and tadpole scalar integrals, respectively. These names clearly
refer to the associated scalar Feynman diagrams; hence, a diagrammatic rep-
resentation of this one-loop decomposition can also be provided. Notice that
the index j encodes the different combinations of the external momenta pi
entering the corresponding qi.

In order to perform this decomposition, it is necessary to reduce tensor
integrals to scalar integrals. Recall that, in a renormalizable theory, the rank
r of a tensor integral of the form given in Eq. (6.1) is bounded by r ≤ N .
Therefore, we shall consider the following tensor integrals, defined with the
same normalization adopted for the scalar integrals above and withD = 4−2ϵ:

A0(m
2
1) =

∫
dDl

(2π)D
µ2ϵ

d1
, (6.4)
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B0; B
µ; Bµν

(
p1;m

2
1,m

2
2

)
=

∫
dDl

(2π)D
µ2ϵ (1; lµ; lµlν)

d1d2
, (6.5)

C0; C
µ; Cµν ; Cµνα

(
p1, p2;m

2
1,m

2
2,m

2
3

)
=

∫
dDl

(2π)D
µ2ϵ (1; lµ; lµlν ; lµlν lα)

d1d2d3
, (6.6)

D0; D
µ; Dµν ; Dµνα; Dµναβ

(
p1, p2, p3;m

2
1,m

2
2,m

2
3,m

2
4

)
=

∫
dDl

(2π)D
µ2ϵ
(
1; lµ; lµlν ; lµlν lα; lµlν lαlβ

)
d1d2d3d4

. (6.7)

where we use a shortened notation for the denominators,

di =

(
l +

i−1∑
k=1

pk

)2

−m2
i , i = 1, . . . , 4. (6.8)

Moreover, we have introduced a factor µ2ϵ = µ4−D, where µ is an arbitrary
mass scale, so that the mass dimensions of the integrals coincide with their
corresponding dimensions in D = 4.

We now introduce an algorithm that allows tensor integrals to be reduced
to combinations of scalar integrals, namely the PV decomposition [52]. We
specialize it to the specific case of a rank-two bubble integral and then apply
it to the gluon self-energy as a hands-on example.

6.1.1 Example: reduction of a rank-two bubble integral

As a simple example of the PV procedure, we consider the massless rank-
two integral

Iµν(p) =

∫
dDℓ

(2π)D
µ2ϵ(ℓ+ p)µℓν

d1d2
, (6.9)

where

d1 = ℓ2, d2 = (ℓ+ p)2. (6.10)

Since pµ is the only external momentum available, Lorentz covariance implies
that the tensor integral can be decomposed as

Iµν(p) = gµν a(p2) + pµpν b(p2), (6.11)

where a(p2) and b(p2) are scalar form factors.
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The two form factors can be determined by contracting Eq. (6.11) with
gµν and pµpν . This gives

gµνI
µν = D a+ p2 b =

∫
dDℓ

(2π)D
µ2ϵ ℓ · (ℓ+ p)

d1d2
≡ I1, (6.12)

pµpνI
µν = p2 a+ p4 b =

∫
dDℓ

(2π)D
µ2ϵ(ℓ · p) [p · (ℓ+ p)]

d1d2
≡ I2. (6.13)

To evaluate the first contraction, we use

ℓ · (ℓ+ p) =
1

2

(
d1 + d2 − p2

)
. (6.14)

Therefore,

I1 =
1

2

∫
dDℓ

(2π)D
µ2ϵ
(

1

d1
+

1

d2
− p2

d1d2

)
= −p

2

2
B0(p; 0, 0). (6.15)

where we used the scalar bubble

B0(p; 0, 0) =

∫
dDℓ

(2π)D
µ2ϵ

ℓ2(ℓ+ p)2
, (6.16)

and that the one-propagator integrals appearing in the first line are scaleless
tadpoles and hence vanish in dimensional regularization.

For the second contraction, one can write

ℓ · p = 1

2

(
d2 − d1 − p2

)
, p · (ℓ+ p) =

1

2

(
d2 − d1 + p2

)
. (6.17)

It follows that

(ℓ · p) [p · (ℓ+ p)] =
1

4

[
(d2 − d1)

2 − p4
]
. (6.18)

Consequently,

I2 =
1

4

∫
dDℓ

(2π)D
µ2ϵ
(
d2
d1

+
d1
d2

− 2− p4

d1d2

)
= −p

4

4
B0(p; 0, 0), (6.19)

where the first three terms vanish because they reduce to scaleless integrals.
The form factors therefore satisfy

(
D p2

p2 p4

)(
a
b

)
=

−p
2

2
B0(p; 0, 0)

−p
4

4
B0(p; 0, 0)

 . (6.20)



66 One-loop amplitudes and generalized unitarity

Solving this system gives

a(p2) =
p2

4(1−D)
B0(p; 0, 0), b(p2) =

D − 2

4(1−D)
B0(p; 0, 0). (6.21)

For a two-point function, there is only one independent external momentum,
so the corresponding Gram matrix is one-dimensional and proportional to p2.
In this context, the standard PV reduction assumes that the Gram matrix
of the independent external momenta is invertible. Exceptional kinematics
with a vanishing Gram determinant must be treated separately, while small
Gram determinants may lead to numerical instabilities. In the present case
the system can be straightforwardly solved:

Iµν(p) =
B0(p; 0, 0)

4(1−D)

[
p2gµν + (D − 2)pµpν

]
. (6.22)

Application to the gluon self-energy As an application of the rank-two
bubble reduction derived above, we consider the fermion-loop contribution to
the gluon self-energy. Among the different one-loop contributions to the gluon
two-point function, this is the one generated by the nf quark flavours circulat-
ing in the loop. We assume that the quarks are massless. The corresponding
diagram is reported in Fig. 6.2.

a, µ b, ν

p

ℓ+ p

ℓ

p

Figure 6.2: Fermion-loop contribution to the gluon self-energy.

Using Tr(tatb) = TF δ
ab, and including the minus sign associated with a

closed fermion loop, the diagram gives

iΠab,µν
q (p) = −g2 nfTF δab Tr

(
γµγαγνγβ

)
Iαβ(p), (6.23)

where

Iαβ(p) =

∫
dDℓ

(2π)D
µ2ϵ (ℓ+ p)αℓβ

ℓ2(ℓ+ p)2
. (6.24)

Using the rank-two bubble reduction derived above, one immediately finds

Iαβ(p) =
B0(p; 0, 0)

4(1−D)

[
p2gαβ + (D − 2)pαpβ

]
, (6.25)

The Dirac algebra and all contracted Lorentz indices are treated in D dimen-
sions, with Tr(1) = 4. Now, using

Tr
(
γµγαγνγβ

)
= 4

(
gµαgνβ − gµνgαβ + gµβgνα

)
, (6.26)
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we obtain

Tr
(
γµγαγνγβ

)
Iαβ(p) =

2(D − 2)

D − 1
B0(p; 0, 0)

(
p2gµν − pµpν

)
. (6.27)

Therefore,

iΠab,µν
q (p) = g2nfTF δ

ab 2(D − 2)

D − 1
B0(p; 0, 0)

(
pµpν − p2gµν

)
. (6.28)

Notice that the result is manifestly transverse:

pµΠ
ab,µν
q (p) = 0. (6.29)

Clearly, this result contains a UV divergence, which must be renormalized in
order for the diagram to be completely finite.

This example illustrates the power of the PV reduction: once we know
how to decompose any tensor integral, it is only a matter of computing scalar
integrals to obtain the desired one-loop amplitude.

6.1.2 Passarino–Veltman reduction pattern

As shown in the previous section, the PV algorithm allows us to decompose
a tensor integral in terms of scalar integrals. We have provided the simple
example of a rank-two tensor bubble integral. In general, a rank-r form factor
of an N -point integral is expressed in terms of lower-rank coefficients of the
same topology and coefficients of integrals with one propagator removed. The
latter are (N−1)-point functions. Repeating the procedure eventually reduces
every tensor integral to scalar tadpole, bubble, triangle, and box integrals. In
Tab. 6.1, we summarize the reduction pattern for all tensor integrals. For
a precise definition of the coefficients appearing in the table, see Ref. [15].
Though we do not explicitly derive all form factors, we summarize through
the following steps the PV reduction algorithm:

• contract the tensor integral with all independent external momenta and,
when necessary, with the metric tensor;

• rewrite the scalar products involving the loop momentum in terms of
inverse propagators and kinematic invariants, allowing propagator-like
denominators to be canceled;

• solve the resulting linear system of equations for the scalar form factors.

By applying these steps recursively, tensor integrals are reduced to lower-rank
tensor integrals and, eventually, to scalar one-loop integrals.
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Form factor Lower-rank form factors and scalar integrals

Dijkl −→ D00ij , Dijk, Cijk, Cij , Ci, C0

D00ij −→ Dijk, Dij , Cij , Ci

D0000 −→ D00i, D00, C00

Dijk −→ D00i, Dij , Cij , Ci

D00i −→ Dij , Di, Ci, C0

Dij −→ D00, Di, Ci, C0

D00 −→ Di, D0, C0

Di −→ D0, C0

Cijk −→ C00i, Cij , Bij , Bi

C00i −→ Cij , Ci, Bi, B0

Cij −→ C00, Ci, Bi, B0

C00 −→ Ci, C0, B0

Ci −→ C0, B0

B11 −→ B00, B1, A0

B00 −→ B1, B0, A0

B1 −→ B0, A0

Table 6.1: Reduction chains in the PV procedure. Tensor form factors of rank r are
expressed in terms of lower-rank form factors and scalar integrals.
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6.2 Implications of unitarity

The basic mathematical object of scattering processes in QFT (quantum
field theory) is the S-matrix. It maps asymptotic incoming states into asymp-
totic outgoing states, after they have interacted in a certain way described by
the underlying theory at play. It is conventionally written as

S = 1 + iT, (6.30)

where T is the transition matrix and contains the non-trivial part of the scat-
tering process. Its matrix elements define the scattering amplitude through

⟨f |T |i⟩ = (2π)4δ(4)(pi − pf )M(i→ f), (6.31)

where pi and pf denote the total initial- and final-state momenta, respectively.
Conservation of probability requires the S-matrix to be unitary,

S†S = 1. (6.32)

Using Eq. (6.30), this condition becomes

1 =
(

1 − iT †
)
(1 + iT ) . (6.33)

Notice that the transition matrix is not, in general, Hermitian: T † ̸= T . To
express Eq. (6.33) in terms of scattering amplitudes, we insert a complete set
of intermediate states,

1 =
∑
x

∫
dΠx |x⟩⟨x|, (6.34)

where the sum runs over all possible intermediate states, including their dis-
crete quantum numbers, and

dΠx =
∏
j∈x

d3pj

(2π)3 2Ej
(6.35)

is the multiparticle phase-space measure.
Taking the matrix element of Eq. (6.33) between ⟨f | and |i⟩, the left-hand

side gives

⟨f |i(T † − T )|i⟩ = i⟨i|T |f⟩∗ − i⟨f |T |i⟩
= i(2π)4δ(4)(pi − pf ) [M

∗(f → i)−M(i→ f)] . (6.36)

The right-hand side instead reads

⟨f |T †T |i⟩ =
∑
x

∫
dΠx ⟨f |T †|x⟩⟨x|T |i⟩

=
∑
x

∫
dΠx (2π)

4δ(4)(pf − px)(2π)
4δ(4)(px − pi)

×M(i→ x)M∗(f → x). (6.37)
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After factoring out the overall momentum-conserving delta function, one ob-
tains the generalized optical theorem,

M(i→ f)−M∗(f → i) = i
∑
x

∫
dΠx (2π)

4δ(4)(pi−px)M(i→ x)M∗(f → x).

(6.38)
Sums over the spin, polarization and internal quantum numbers of the inter-
mediate particles are implicit.

For forward scattering, f = i, the generalized relation reduces to the well-
known optical theorem:

2 ImM(i→ i) =
∑
x

∫
dΠx (2π)

4δ(4)(pi − px) |M(i→ x)|2 . (6.39)

An important feature of this equation is that it relates the imaginary part
of a scattering amplitude to products of amplitudes of lower perturbative
order. This relation provides the theoretical basis of unitarity-cut methods,
in which selected internal propagators are placed on shell and a loop amplitude
is reconstructed from products of on-shell amplitudes.

If the initial state consists of a single particle A, its partial decay width
into an arbitrary multiparticle state x is

Γ(A→ x) =
1

2mA

∫
dΠx (2π)

4δ(4)(pA − px) |M(A→ x)|2 . (6.40)

It then follows from Eq. (6.39) that

ImM(A→ A) = mA

∑
x

Γ(A→ x) = mAΓtot. (6.41)

Similarly, for a two-particle initial state A = a+ b, the total cross-section
in the centre-of-mass frame is related to the forward scattering amplitude by

ImM(A→ A) = 2ECM|pi|
∑
x

σ(A→ x), (6.42)

which is the usual optical theorem for the forward cross-section.
Now, Eq. (6.39) admits a simple diagrammatic interpretation which we

report in Eq. (6.43): the imaginary part of a scattering amplitude can be
obtained by summing over all possible on-shell intermediate states x that cut
the diagram into two lower-order amplitudes.

2 Im

i


 f

 =
∑
x

∫
dΠx

i


x

x


 f

 .

(6.43)
The precise connection between the imaginary part of an amplitude and

unitarity cuts, are given by the cutting rules [2] that can be summarized as
follows:



One-loop amplitudes and generalized unitarity 71

1. Cut the diagram in every possible way such that all cut propagators can
be simultaneously placed on shell without violating momentum conser-
vation.

2. For each cut propagator, perform the replacement

1

p2 −m2 + iϵ
−→ −2πi δ

(
p2 −m2

)
θ
(
p0
)
. (6.44)

3. Sum over all possible cuts.

4. The resulting expression gives the discontinuity of the diagram, with

Disc(iM) ≡ lim
ϵ→0+

[iM(s+ iϵ)− iM(s− iϵ)] = −2 ImM. (6.45)

Notice that rule number 2 provides a precise physical interpretation of a
unitarity cut: cutting a propagator means placing the corresponding particle
on shell. This is indeed enforced by the Dirac delta function, which requires
that p2 = m2 [53].

Relation between optical theorem and unitarity cuts: the muon
decay. As a simple example of the relation between the optical theorem
and unitarity cuts, let us consider muon decay in the Fermi theory, including
only QED corrections. The effective Lagrangian of interest reads

LCC
Fermi = − 4GF√

2

[
(ēLγ

µµL)(ν̄µ,Lγµνe,L) + (µ̄Lγ
µeL)(ν̄e,Lγµνµ,L)

]
. (6.46)

Here, terms involving only muonic or electronic fields have been neglected,
and the Fierz identity [2] has been applied. The first term in Eq. (6.46) can
annihilate a left-handed muon and create a left-handed electron together with
a muon neutrino and a right-helicity electron antineutrino state created by the
left-chiral neutrino field. This generates Feynman diagrams in which the muon
is annihilated. By similar reasoning, the second term in the Lagrangian, i.e.
its Hermitian conjugate, is also required, as it generates Feynman diagrams
in which the outgoing muon is created. We will need both contributions for
the purposes of this section.

The optical theorem for forward muon scattering reads

2 ImM(µ→ µ) =
∑
X

∫
dΠX (2π)4δ(4)(pµ − pX)

∣∣M(µ→ X)
∣∣2. (6.47)

In the present case the sum over intermediate states naturally includes

X = {X0 = e− ν̄e νµ, X1 = e− ν̄e νµ γ, ...}. (6.48)

Suppose we are interested in the QED corrections up to relative order α.
Then, it is sufficient to retain the first two decay channels, namely the three-
particle state X0 and the four-particle state X1. The inclusion of both virtual
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corrections to X0 and real-photon emission through X1 is also required for the
cancellation of infrared divergences, in accordance with the KLN theorem [2].

Let us focus on the process M(µ → X0) only. This can be expanded in
the following way

M(µ→ X0) = M0 +Mvirt + O(α2), (6.49)

where M0 is the tree-level Fermi amplitude, while Mvirt denotes the one-loop
QED virtual correction at first order in α. In relative power counting one has

M0 ∼ O(1), Mvirt ∼ O(α). (6.50)

From a diagrammatic point of view we have

M(µ→ X0) = µ− e−

νµ

ν̄e︸ ︷︷ ︸
M0

+ µ− e−

νµ

ν̄e︸ ︷︷ ︸
Mvirt

+ O(α2).

(6.51)
Since the optical theorem holds at any order in perturbation theory, we

can write that at relative order O(1) we have

2 ImM(µ→ µ)
∣∣∣
O(1)

=

∫
dΠX0 (2π)

4δ(4)(pµ − pX0)
∣∣M0

∣∣2. (6.52)

Conversely, at relative order O(α) the optical theorem yields

2 ImM(µ→ µ)
∣∣∣
O(α)

=

∫
dΠX0 (2π)

4δ(4)(pµ − pX0)
[
M0M

∗
virt +MvirtM

∗
0

]
+

(∫
dΠX1 (2π)

4δ(4)(pµ − pX1)
∣∣M(µ− → X1)

∣∣2) ∣∣∣
O(α)

.

(6.53)

The two interference terms are precisely the virtual corrections of relative
order α.

Let us now make contact with unitarity cuts. The O(1) relation in Eq. (6.52),
contains the squared modulus of M0, which directly corresponds to a three-
particle cut through the X0 intermediate state. Hence, Eq. (6.52) has the
following diagrammatic interpretation

2 ImM(µ→ µ)
∣∣∣
O(1)

∼ µ µ
e

νµ

νe

. (6.54)
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Conversely, let us consider Eq. (6.53). The first line corresponds to two
different three-particle cuts which pass through the X0 intermediate state and
contains the virtual QED correction to the decay. The second line corresponds
instead to the four-particle cuts and represents real photon emission, µ →
e ν̄e νµγ, namely the X1 intermediate state. In the present discussion we only
focus on the first contribution. Explicitly, Eq. (6.53) naturally allows for the
following diagrammatic interpretation

2 ImM(µ→ µ)
∣∣∣
O(α)

∼ µ µ
e

νµ

νe

+ µ µ
e

νµ

νe

+
(
4-particle cuts

)
.

(6.55)

In summary, this example explicitly illustrates the connection between the
optical theorem and unitarity cuts. The imaginary part of the forward ampli-
tude µ→ µ is obtained by summing over all allowed on-shell cuts. At order α,
the three-particle cuts reproduce the interference between the tree-level decay
amplitude and the virtual QED corrections, while the four-particle cuts ac-
count for real photon emission. This is the simplest manifestation, within the
Fermi theory, of the general statement that cuts extract the discontinuity of
a loop amplitude and relate it to products of lower-order on-shell amplitudes.

6.3 Generalized unitarity

Up to this point, we have explored the relation between the imaginary part
of an amplitude and on-shell unitarity cuts. In this section, we see how the
latter can provide further insights into the structure of a scattering amplitude.

We refer to this extension as generalized unitarity. The basic idea is that,
by taking more than one cut of a one-loop amplitude, we can reconstruct
its complete behaviour in terms of the scalar integrals defined in Eqs. (6.4),
(6.5), (6.6), and (6.7), thus bypassing the PV-reduction algorithm. Multiple
cuts indeed act as projectors onto specific integral topologies and can be used
to determine their coefficients recursively. In order to illustrate the working
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principle schematically, we consider a 4-point amplitude and decompose it in
terms of scalar integrals:

M = d + c + b + a . (6.56)

Notice that the above decomposition matches the one reported in Eq. (6.3),
but this time the scalar integrals are sketched as Feynman diagrams. Actually,
in this expansion we are missing the rational term R, which requires more care
to be extracted and will be discussed in the following sections.

Let us now exploit generalized unitarity with the aim of finding all the
coefficients multiplying the different topologies. We first cut as many inter-
nal propagators as possible; in this case, we should perform a quadruple cut.
Clearly, this puts four internal propagators on shell. By cutting the left-hand
side of Eq. (6.56) along its four internal propagators, only one term in the
expansion on the right-hand side survives, namely the box contribution. This
is because, in the case of the triangle, bubble, and tadpole topologies, we can-
not possibly take four cuts, since there are not enough internal propagators.
Diagrammatically, this translates into:

M = d
find−−→ d. (6.57)

Let us consider now triple cuts. This time, cutting through three internal
propagators is allowed for both the box and triangle integrals. Since the triple
cut is shared by the box and triangle topologies, we can obtain the coefficient
c by subtracting from the triple cut of M the remaining contribution from
the triple cut of the box diagram. Diagrammatically, this can be written as
follows:

M = d + c

find−−→ c.

(6.58)

Similarly, a double cut receives contributions from boxes, triangles and
bubbles. After subtracting the already known box and triangle contributions,
the remaining term determines the bubble coefficient b:

M = d + c

+ b
find−−→ b.

(6.59)
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Finally, a single cut can receive contributions from all the integral topolo-
gies. Once the coefficients d, c and b have been determined, their contributions
can be removed and the remaining term isolates the coefficient a:

M = d + c

+ b + a
find−−→ a.

(6.60)

The derivation of the coefficients is clearly recursive. In particular, cutting
the highest possible number of internal propagators is usually relatively easy
from a computational point of view. However, going down to the tadpole
contributions requires much more care, and therefore an automation through
some software is usually preferred.

We will apply this mechanism to the evaluation of the gluon-fusion Higgs
production process, in which we implement this cut construction of the am-
plitude by means of a Mathematica [26] package called SMaSH [27].

A convenient way of exploiting the generalized unitarity method just out-
lined, is by expanding the loop momentum in some four-momentum basis
before taking the cuts. This is because, as prescribed in Eq. (6.44), taking
a cut means substituting an internal propagator with a delta function whose
argument p2 − m2 depends on the loop momentum of the amplitude itself.
If we manage to parametrize the loop momentum in some basis, each delta
function basically constrains one of the coefficients of this expansion. In this
way, the set of delta functions in the loop integral, which corresponds to the
set of propagators that have been cut, allows us to determine the constrained
loop momentum that can flow through the cut diagram. We will see that
this point significantly reduces the computational effort, since, in the end, we
will not need to perform the actual loop integrals, but only to determine the
constraints on the loop momentum imposed by the Dirac delta functions.

The central point is: in which basis should we expand the loop momen-
tum? The answer is actually not trivial, since it generally depends on both
the dimensionality of spacetime, which plays a fundamental role in the de-
termination of the rational term R, and the external momenta involved in
the process. In the following section, we will provide the fundamental tools
needed to perform this loop-momentum expansion.

6.3.1 The van Neerven–Vermaseren basis

The implementation of generalized unitarity requires a convenient parametriza-
tion of the loop momentum. In particular, it is useful to separate the compo-
nents of the loop momentum that are determined by the external kinematics
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from those belonging to the transverse space. The van Neerven–Vermaseren
basis provides a natural framework for performing this decomposition [54].

A fundamental constraint is provided by the Schouten identity. In 4-
dimensional space-time, a totally antisymmetric rank-five tensor necessarily
vanishes since 2 of its indices must be repeated. Therefore, in D = 4 the
following holds

ℓλϵµ1µ2µ3µ4 = ℓµ1ϵλµ2µ3µ4 + ℓµ2ϵµ1λµ3µ4

+ ℓµ3ϵµ1µ2λµ4 + ℓµ4ϵµ1µ2µ3λ,
(6.61)

where l is the loop momentum. We use this relation as the starting point of
the discussion as it makes the linear dependence of sufficiently large sets of
momenta explicit.

We will actually only present the result of the expansion of the loop mo-
mentum in D-dimensions, while showing the working mechanism in a simpler
situation, namely in a 2-dimensional space-time.

The two-dimensional basis. To introduce the basic idea, consider a two-
dimensional vector space spanned by two linearly independent, but not or-
thogonal, vectors qµ1 and qµ2 . Their linear independence requires

ϵq1q2 ≡ ϵµνq1,µq2,ν ̸= 0. (6.62)

If q1 and q2 were parallel, ϵq1q2 would vanish and they would not span the
two-dimensional space, so the construction below would not be well defined.
An arbitrary vector ℓµ belonging to this space can be written as

ℓµ = c1q
µ
1 + c2q

µ
2 . (6.63)

However, since q1 and q2 are not orthogonal, the coefficients ci cannot be
obtained directly by contracting ℓµ with qµi . For instance,

q1 · ℓ = c1q
2
1 + c2(q1 · q2), (6.64)

which depends on both coefficients.
Let us consider the Schouten identity in two dimensions

ℓλϵµν = ℓµϵλν + ℓνϵµλ. (6.65)

Contracting this equation with q1,µq2,ν , one obtains

ℓλϵq1q2 = (ℓ · q1)ϵλq2 + (ℓ · q2)ϵq1λ. (6.66)

It is therefore natural to introduce the dual vectors

vλ1 ≡ ϵλq2

ϵq1q2
, vλ2 ≡ ϵq1λ

ϵq1q2
, (6.67)
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in terms of which

ℓλ = (ℓ · q1)vλ1 + (ℓ · q2)vλ2 , (6.68)

which is obtained from Eq. (6.66) by dividing by ϵq1q2 . The two sets of vectors
are dual, since

vi · qj = δij . (6.69)

The vectors vµi are not, in general, orthonormal among themselves,

vi · vj ̸= δij . (6.70)

Nevertheless, they define a useful coordinate system because the coefficient
of vµi in Eq. (6.68) is precisely the projection ℓ · qi.

Suppose now that the vectors qi appear as shifts of the loop momentum
in the inverse propagators

di = (ℓ+ qi)
2 −m2

i , d0 = ℓ2 −m2
0, q0 = 0. (6.71)

Here, we are clearly still referring to the momentum configuration presented
in Fig. 6.1, where the vectors qi are combinations of the external momenta
pi. The difference between the two denominators read

di − d0 = 2ℓ · qi + q2i −m2
i +m2

0, (6.72)

and hence

ℓ · qi =
1

2

[
di − d0 − q2i +m2

i −m2
0

]
. (6.73)

This is the crucial property of the basis: factors of the loop momentum along
the physical directions can be traded for differences of inverse propagators,
which may subsequently cancel against the denominators of the integrand.

The same construction can be reformulated without explicitly referring
to the Levi–Civita tensor in order to set the stage for arbitrary dimensional
space-time. First, in two dimensions, we can use the identity

ϵµ1µ2ϵν1ν2 = δµ1µ2
ν1ν2 , (6.74)

with all other components fixed by antisymmetry. where the rank-two gener-
alized Kronecker symbol is defined as

δµ1µ2
ν1ν2 ≡ det

(
δµ1
ν1 δµ1

ν2

δµ2
ν1 δµ2

ν2

)
= δµ1

ν1 δ
µ2
ν2 − δµ1

ν2 δ
µ2
ν1 . (6.75)

We can now rewrite the dual vectors introduced in Eq. (6.67). Starting
from

vµ1 =
ϵµq2

ϵq1q2
, (6.76)
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we multiply both numerator and denominator by ϵq1q2 , obtaining

vµ1 =
ϵq1q2 ϵ

µq2

ϵq1q2 ϵ
q1q2

=
ϵρσϵ

µνqρ1q
σ
2 q2,ν

ϵρσϵαβq
ρ
1q

σ
2 q1,αq2,β

.

(6.77)

Using Eq. (6.74), the numerator becomes

ϵρσϵ
µνqρ1q

σ
2 q2,ν = δµνρσ q

ρ
1q

σ
2 q2,ν

≡ δµq2q1q2 .
(6.78)

Expanding the generalized Kronecker symbol explicitly,

δµq2q1q2 =
(
δµρ δ

ν
σ − δµσδ

ν
ρ

)
qρ1q

σ
2 q2,ν

= qµ1 q
2
2 − qµ2 (q1 · q2). (6.79)

Similarly,
δq1µq1q2 = q21q

µ
2 − (q1 · q2)qµ1 . (6.80)

Whereas, the common denominator reads

∆2 ≡ ϵq1q2ϵ
q1q2

= δq1q2q1q2

= δµνρσ q1,µq2,νq
ρ
1q

σ
2

=
(
δµρ δ

ν
σ − δµσδ

ν
ρ

)
q1,µq2,νq

ρ
1q

σ
2

= q21q
2
2 − (q1 · q2)2.

(6.81)

This is precisely the so-called Gram determinant associated with the two
vectors q1 and q2.

The dual vectors can therefore be written as

vµ1 =
δµq2q1q2

∆2
=
q22q

µ
1 − (q1 · q2)qµ2

q21q
2
2 − (q1 · q2)2

, vµ2 =
δq1µq1q2

∆2
=
q21q

µ
2 − (q1 · q2)qµ1

q21q
2
2 − (q1 · q2)2

.

(6.82)
The duality relations can now be verified directly. For instance,

v1 · q1 =
q22q

2
1 − (q1 · q2)2

∆2
= 1, (6.83)

v1 · q2 =
q22(q1 · q2)− (q1 · q2)q22

∆2
= 0, (6.84)

and analogously
v2 · q1 = 0, v2 · q2 = 1. (6.85)

Hence,
vi · qj = δij . (6.86)
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In what sense are we avoiding using the Levi-Civita tensor in this new con-
struction? Notice that though Eq. (6.74) holds in a 2-dimensional space-time
only, the generalized Kronecker symbol δµ1µ2

ν1ν2 can be easily extended up to a
n-dimensional space-time. Explicitly, we have shifted from the dual vectors in
Eq. (6.67) defined using the ϵ tensor, to those in Eq. (6.82), which can belong
to any chosen dimensional space-time. This is important since it allows the
construction to be extended to generic one-loop configurations.

Before seeing how the van Neerven–Vermaseren decomposition makes it
particularly convenient to impose generalized unitarity conditions, we first
need to provide the D-dimensional extension of the case just discussed.

Physical and transverse spaces. We now consider a generic N -particle
scattering amplitude in a renormalizable quantum field theory inD-dimensional
space-time. Each one-loop Feynman diagram contributing to the amplitude
can be described by an integrand of the form

IN (p1, . . . , pN ; ℓ) =
NI(p1, . . . , pN ; ℓ)

d1d2 · · · dR
, (6.87)

where R denotes the number of loop-momentum-dependent propagators and

di = (ℓ+ qi)
2 −m2

i , i = 1, . . . , R, (6.88)

where we are slightly changing the notation with respect to the one adopted
in the previous section. The vectors qi will be referred to as the propagator
momenta.

Associated with the R propagators there is a set of R inflow momenta ki,
defined by

ki = qi − qi−1. (6.89)

The ki are either external momenta pj or linear combinations of them,

ki =
N∑
j=1

αijpj , (6.90)

where the coefficients αij depend on the particular diagram. Momentum
conservation implies

R∑
i=1

ki = 0. (6.91)

A suitable diagrammatic representation is shown in Fig. 6.31.
The vector space spanned by the inflow momenta ki is called the physical

space. Since Eq. (6.91) implies that at most R − 1 of them are linearly
independent, its dimension is

DP = min(D,R− 1). (6.92)

1With respect to Fig. 6.1 we use the notation adopted in this section
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k1

k2

k3
k4

kR−1

kR

l + qR

l + q1

l + q2 l + q3

l + qR−1

m1

m2

m3 m4

mN

...

Figure 6.3: Generic one-loop N -point diagram. All external momenta are taken to
be incoming.

The orthogonal complement of the physical space defines the transverse space,
whose dimension is therefore

DT = D −DP = max(0, D − (R− 1)). (6.93)

Thus,
D = DP +DT . (6.94)

In particular, if R > D, the physical space spans the entire D-dimensional
space and

DT = 0. (6.95)

This was the case of the 2-dimensional parametrization provided above. The
inflow momenta define a natural, although in general non-orthogonal, coor-
dinate system in the physical space. In order to construct the corresponding
dual basis, we introduce the generalized Kronecker symbol

δµ1···µs
ν1···νs ≡ det


δµ1
ν1 δµ1

ν2 · · · δµ1
νs

δµ2
ν1 δµ2

ν2 · · · δµ2
νs

...
...

. . .
...

δµs
ν1 δµs

ν2 · · · δµs
νs

 . (6.96)

The Gram determinant associated with a set of s vectors is then defined as

∆(k1, . . . , ks) ≡ δk1···ksk1···ks = det(ki · kj) . (6.97)

The generalized Kronecker symbol vanishes whenever the number of anti-
symmetrized indices exceeds the dimensionality of the vector space. For the
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special case in which the number of indices equals D, it can be expressed in
terms of two Levi–Civita tensors,

δµ1···µD
ν1···νD = ϵµ1···µDϵν1···νD , (6.98)

up to the sign convention associated with the metric and the Levi–Civita
tensor.

We can now construct the van Neerven–Vermaseren basis of the physi-
cal space. Choosing DP independent inflow momenta, the dual vectors are
defined by

vµi (k1, . . . , kDP
) ≡

δ
k1···ki−1 µki+1···kDP
k1···ki−1 ki ki+1···kDP

∆(k1, . . . , kDP
)

, i = 1, . . . , DP , (6.99)

where we simply generalized what we found in Eq. (6.82). By construction,
these vectors satisfy

vi · kj = δij , i, j = 1, . . . , DP . (6.100)

The vectors vµi therefore constitute the basis dual to the independent inflow
momenta kµi . This property is especially useful because the coefficient of each
vµi in the decomposition of an arbitrary vector is simply its projection onto
kµi .

When R ≤ D, it is useful to introduce the projector onto the transverse
space,

wµ
ν(k1, . . . , kR−1) ≡

δ
k1···kR−1ν
k1···kR−1µ

∆(k1, . . . , kR−1)
. (6.101)

It satisfies the standard properties of a projection operator,

wµ
µ = DT = D + 1−R, kµi wµν = 0, wµ

αw
αν = wµν . (6.102)

We denote by
nµr , r = 1, . . . , DT , (6.103)

an orthonormal basis of the transverse space. These vectors satisfy

nr · ns = δrs, ki · nr = 0, vi · nr = 0, (6.104)

and the transverse metric can be written as

wµν =

DT∑
r=1

nµrn
ν
r . (6.105)

The full D-dimensional metric tensor can consequently be decomposed
into its physical and transverse components,

gµν =

DP∑
i=1

kµi v
ν
i + wµν , (6.106)
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or, equivalently,

gµν =

DP∑
i=1

kµi v
ν
i +

DT∑
r=1

nµrn
ν
r . (6.107)

We can now apply this decomposition directly to the loop momentum.
Contracting Eq. (6.107) with ℓν gives

ℓµ =

DP∑
i=1

(ℓ · ki)vµi +

DT∑
r=1

(ℓ · nr)nµr . (6.108)

The first term contains the components of the loop momentum in the physical
space, whereas the second term contains its transverse components.

The physical projections can be expressed directly in terms of inverse
Feynman propagators. Using

di = (ℓ+ qi)
2 −m2

i , di−1 = (ℓ+ qi−1)
2 −m2

i−1, (6.109)

together with
ki = qi − qi−1, (6.110)

we obtain

di − di−1 = 2ℓ · (qi − qi−1) + q2i − q2i−1 −m2
i +m2

i−1

= 2ℓ · ki + q2i − q2i−1 −m2
i +m2

i−1. (6.111)

Therefore,

ℓ · ki =
1

2

[
di − di−1 −

(
q2i −m2

i

)
+
(
q2i−1 −m2

i−1

)]
. (6.112)

Substituting Eq. (6.112) into Eq. (6.108), the loop momentum can be
written as

ℓµ = V µ
R +

1

2

DP∑
i=1

(di − di−1)v
µ
i +

DT∑
r=1

(ℓ · nr)nµr , (6.113)

where

V µ
R = −1

2

DP∑
i=1

[(
q2i −m2

i

)
−
(
q2i−1 −m2

i−1

)]
vµi . (6.114)

Here the cyclic convention

d0 = dR, m0 = mR (6.115)

is understood.
Equation (6.113) is the central result for the applications that follow. The

components of the loop momentum along the physical space are expressed
in terms of inverse propagators, while only the projections onto the trans-
verse directions remain irreducible. Consequently, once a set of propagators
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is placed on shell, the corresponding conditions di = 0 directly constrain the
physical components of the loop momentum.

In fact, a particularly useful feature of the van Neerven–Vermaseren basis
is that it provides a natural parametrization of one-loop integrands in terms of
a restricted set of irreducible loop-momentum structures. In a renormalizable
theory, this allows the integrand to be organized as a linear combination
of terms containing four, three, two, or one Feynman denominators, with
numerators of a highly constrained polynomial form.

Moreover, the same decomposition makes it particularly convenient to
impose generalized unitarity conditions. Once the loop momentum has been
separated into its physical and transverse components, the solutions satis-
fying quadruple-, triple-, double-, and single-cut on-shell conditions can be
constructed systematically. The van Neerven–Vermaseren basis therefore
provides a natural bridge between integrand reduction and generalized D-
dimensional unitarity.

We provide a 2-dimensional example to illustrate these two features of the
van Neerven–Vermaseren basis.

A rank-two bubble and the connection with unitarity. Let us con-
sider a rank-two two-point integrand in 2-dimensional space-time,

Ĩ(k,m1,m2) =
(n̂ · l)2

d1d2
, (6.116)

where
d1 = l2 −m2

1, d2 = (l + k)2 −m2
2, (6.117)

and
n̂ · k = 0, k2 ̸= 0, n̂2 = 1. (6.118)

Since n̂µ is orthogonal to the only independent external momentum kµ, it
spans the transverse space of the corresponding two-point function.

The rank-two two-point function in two dimensions is UV divergent. We
therefore regularize it by analytically continuing the loop momentum to

D = 2− 2ϵ. (6.119)

As the basis vector of the physical space, we choose

nµ =
kµ√
k2
, n2 = 1. (6.120)

Together with n̂µ, it satisfies

nµnν + n̂µn̂ν = gµν(2), (6.121)

where gµν(2) denotes the metric tensor of the two-dimensional subspace. Con-
tracting this relation with lµlν

(n̂ · l)2 = l2(2) − (n · l)2 = l2(2) −
(l · k)2

k2
. (6.122)
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Now, in order to decompose the loop momentum we exploit Eq. (6.107),
also accounting for the extra-dimensional contribution:

lµ = (l · n)nµ + (l · n̂)n̂µ + (l · nϵ)nµϵ , (6.123)

where nµϵ parametrizes the additional (D−2)-dimensional space. Accordingly,

l2 = l2(2) + (nϵ · l)2 = l2(2) + l2ϵ , l2ϵ ≡ (nϵ · l)2. (6.124)

Thus, besides the physical and transverse two-dimensional components, the
loop momentum contains an additional component which disappears if the
calculation is performed strictly in two dimensions.

The scalar products entering Eq. (6.122) can again be expressed through
the inverse propagators. From Eq. (6.117), one obtains

l2(2) = d1 +m2
1 − µ2, 2l · k = d2 − d1 − r21, (6.125)

where we define

r21 = k2 +m2
1 −m2

2, r22 = k2 +m2
2 −m2

1, (6.126)

Using these relations, the original integrand can be rewritten as

Ĩ(k,m1,m2) =
(n̂ · l)2

d1d2

= −λ
2 + l2ϵ
d1d2

+
1

4k2

[
r21 − 2l · k

d1
+
r22 + 2l · k + 2k2

d2

]
.

(6.127)

where

λ2 =
k4 − 2k2(m2

1 +m2
2) + (m2

1 −m2
2)

2

4k2
. (6.128)

This already shows the structure expected from integrand reduction: a two-
propagator contribution accompanied by two one-propagator contributions.
Up to now, we have shown how the van Neerven–Vermaseren basis can be
exploited in order to reduce one-loop integrands to a linear combination of
terms containing Feynman denominators.

Actually, even without knowing Eq. (6.127), we could have started with a
general ansatz of the form

(n̂ · l)2

d1d2
=
b0 + b1(n̂ · l) + b2(nϵ · l)2

d1d2

+
a1,0 + a1,1(n · l) + a1,2(n̂ · l)

d1

+
a2,0 + a2,1(n · l) + a2,2(n̂ · l)

d2
.

(6.129)
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Comparing this parametrization with Eq. (6.127), one immediately finds

b0 = −λ2, b1 = 0, b2 = −1, (6.130)

and

a1,0 =
r21
4k2

, a1,1 = − 1

2
√
k2
, a1,2 = 0,

a2,0 =
r22
4k2

+
1

2
, a2,1 =

1

2
√
k2
, a2,2 = 0.

(6.131)

What can be shown is that the same coefficients can be obtained with-
out performing the explicit algebraic reduction, but by exploiting generalized
unitarity. We provide the computation for the b-coefficients. Multiplying
Eq. (6.129) by d1d2, we obtain

(n̂ · l)2 =
[
b0 + b1(n̂ · l) + b2(nϵ · l)2

]
+ [a1,0 + a1,1(n · l) + a1,2(n̂ · l)] d2
+ [a2,0 + a2,1(n · l) + a2,2(n̂ · l)] d1.

(6.132)

To isolate the b-coefficients, we choose special values of the loop momen-
tum satisfying

d1(l) = d2(l) = 0. (6.133)

In this way, the terms proportional to d1 and d2 vanish identically, so that
only the residue associated with the two-point topology survives. Setting
these Feynman denominators to zero has precisely the meaning of putting the
two propagators on shell of the bubble diagram associated with the integrand
under study. Diagrammatically, this is precisely what we did in Eq. (6.59),
except that here we do not have higher-point cut topologies to subtract.

For the moment, let us restrict the loop momentum to the two-dimensional
subspace by setting

nϵ · l = 0. (6.134)

Imposing the above cut conditions on the loop momentum of Eq. (6.123), two
solutions emerge

l±c = αcn± iβcn̂, (6.135)

where

αc = − r21

2
√
k2
, βc = λ. (6.136)

In particular,
n̂ · l±c = ±iλ. (6.137)

Substituting the two solutions into Eq. (6.132) gives

b0 + b1(n̂ · l+c ) = −λ2, b0 + b1(n̂ · l−c ) = −λ2, (6.138)

from which
b0 = −λ2, b1 = 0, (6.139)
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which correctly reproduce the first two coefficients of the integrand reduction.
Let us now consider the coefficient b2. This coefficient cannot be deter-

mined from a strictly two-dimensional loop momentum, since in this case
nϵ · l = 0. To determine it, we must allow the loop momentum to probe the
additional (D − 2)-dimensional space. The cut conditions remain the same,
but we choose instead

l± = αcn± iβcnϵ. (6.140)

This is obtained from Eq. (6.135) simply by replacing n̂→ nϵ. The conditions

n̂ · l± = 0, (nϵ · l±)2 = −λ2, (6.141)

hold. Equation (6.132) therefore gives

0 = b0 − b2λ
2. (6.142)

Using b0 = −λ2, we obtain

b2 = −1. (6.143)

The coefficients associated with the one-propagator terms can be deter-
mined analogously by imposing a single-cut condition. For example, the co-
efficients a1,i are isolated by requiring

d1(l) = 0, d2(l) ̸= 0, (6.144)

while the coefficients a2,i follow from the opposite choice. We do not display
the calculation here for brevity; see Ref. [15] for the derivation.

The point of this discussion was to make the connection between integrand
reduction and unitarity particularly transparent. The coefficients of the dif-
ferent integral topologies are obtained by evaluating the integrand at special
values of the loop momentum for which selected inverse Feynman propagators
vanish. Since

di(l) = 0 (6.145)

is precisely the on-shell condition for the corresponding internal particle, the
algebraic projection onto a given residue is naturally interpreted as a gener-
alized unitarity cut.

Moreover, the role of the D-dimensional loop momentum is already visible
in this simple example. In particular, the structure

(nϵ · l)2

d1d2
(6.146)

cannot be detected by restricting l to the original two-dimensional space. The
continuation of the loop momentum to D = 2 − 2ϵ dimensions is therefore
essential to reconstruct this contribution. The analogous extra-dimensional
structures in four-dimensional calculations are precisely responsible for con-
tributions to the rational part of one-loop amplitudes.
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6.3.2 Integrand reduction in D dimensions

We now extend the previous discussion to D-dimensional space-time. The
aim is not to reproduce the complete derivation of the reduction procedure,
but rather to introduce the general parametrization of a one-loop integrand
and to emphasize the role played by the D-dimensional loop momentum. This
construction is known as OPP parametrization [15,55]. We consider a generic
one-loop integral of the form

IN =

∫
dDl

(2π)D
Num(l)∏
i

di(l)
, (6.147)

where
di(l) = (l + qi)

2 −m2
i (6.148)

are the inverse Feynman propagators. We can decompose the numerator in
the following suggestive way

IN =

∫
dDl

(2π)D
1∏

i

di(l)

{ ∑
i1,i2,i3,i4,i5

ẽi1i2i3i4i5(l)
∏

j /∈{i1,i2,i3,i4,i5}

dj(l)

+
∑

i1,i2,i3,i4

d̃i1i2i3i4(l)
∏

j /∈{i1,i2,i3,i4}

dj(l)

+
∑

i1,i2,i3

c̃i1i2i3(l)
∏

j /∈{i1,i2,i3}

dj(l)

+
∑
i1,i2

b̃i1i2(l)
∏

j /∈{i1,i2}

dj(l)

+
∑
i1

ãi1(l)
∏
j ̸=i1

dj(l)

}
.

(6.149)

The functions ẽ, d̃, c̃, b̃, and ã are respectively associated with five-, four-,
three-, two-, and one-point functions.

An important feature of Eq. (6.149) is that, in the present discussion, all
inverse propagators appear only to the first power. More generally, higher
powers of propagators may arise, for instance in particular expansions or
in multi-loop calculations after IBP reduction, but such cases will not be
considered here. Therefore, by choosing special values of the loop momentum
for which different subsets of inverse propagators vanish, one can project
directly onto the corresponding functions. This is precisely the point at which
integrand reduction naturally connects with generalized unitarity.

Parametrization of the loop momentum. The van Neerven–Vermaseren
basis introduced in the previous section provides a convenient way of deter-
mining the allowed l-dependence of the functions appearing in Eq. (6.149).
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Consider first a five-point function with propagators

di(l) = (l + qi)
2 −m2

i , i = 0, . . . , 4, q0 = 0. (6.150)

The four vectors q1, . . . , q4 span the four-dimensional physical space. The
loop momentum is therefore decomposed as

lµ =
4∑

i=1

(l · qi)vµi + (l · nϵ)nµϵ . (6.151)

The first term contains the four-dimensional components of the loop momen-
tum, whereas nµϵ parametrizes its extra-dimensional component.

As before, the physical projections are directly related to inverse propa-
gators,

l · qi =
1

2

[
di − d0 −

(
q2i −m2

i +m2
0

)]
. (6.152)

Consequently, the dependence of a numerator on the physical components
of lµ can be systematically traded for inverse propagators. What remains
after this procedure are irreducible scalar products involving the transverse
components of the loop momentum.

For a rank-five five-point function, repeated application of Eq. (6.152)
shows that the corresponding five-point residue contains no irreducible de-
pendence on l,

ẽ01234(l) = ẽ
(0)
01234. (6.153)

For a four-point function, the physical space is three-dimensional. The
loop momentum is decomposed as

lµ =

3∑
i=1

vµi (l · qi) + (l · n4)nµ4 + (l · nϵ)nµϵ , (6.154)

where nµ4 spans the four-dimensional transverse space. For tensor integrals of
rank not higher than four, the most general four-point residue can be written
as [15]

d̃0123(l) = d̃0 + d̃1(l · n4) + d̃2(l · nϵ)2

+ d̃3(l · nϵ)2(l · n4) + d̃4(l · nϵ)4.
(6.155)

For a three-point function, the physical space is two-dimensional and the
four-dimensional transverse space is also two-dimensional. Thus,

lµ =
2∑

i=1

vµi (l · qi) + (l · n3)nµ3 + (l · n4)nµ4 + (l · nϵ)nµϵ . (6.156)

Taking into account the relations among the different transverse components,
the corresponding residue may be parametrized as

c̃012(l) = c̃0 + c̃1(l · n3) + c̃2(l · n4) + c̃3
[
(l · n3)2 − (l · n4)2

]
+ c̃4(l · n3)(l · n4) + c̃5(l · n3)3 + c̃6(l · n4)3

+ c̃7(l · nϵ)2 + c̃8(l · nϵ)2(l · n3) + c̃9(l · nϵ)2(l · n4).
(6.157)
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Similar considerations determine the parametrization of the two-point and
one-point functions. For a rank-two two-point function one finds

b̃01(l) = b̃0 + b̃1(l · n2) + b̃2(l · n3) + b̃3(l · n4)

+ b̃4
[
(l · n2)2 − (l · n4)2

]
+ b̃5

[
(l · n3)2 − (l · n4)2

]
+ b̃6(l · n2)(l · n3) + b̃7(l · n3)(l · n4)

+ b̃8(l · n2)(l · n4) + b̃9(l · nϵ)2,

(6.158)

while the general numerator of a one-point function is

ãi(l) = ã0 + ã1(l · n1) + ã2(l · n2) + ã3(l · n3) + ã4(l · n4). (6.159)

make an important feature of integrand reduction explicit. The dependence on
the loop momentum is highly constrained: after all reducible scalar products
have been expressed through inverse propagators, only a finite number of
irreducible transverse structures remain.

The precise polynomial degree appearing in the previous expressions is
a consequence of the maximal tensor rank allowed in a renormalizable the-
ory. In an effective field theory, higher-rank numerators can occur, and the
parametrizations must be enlarged accordingly. The logic of the construction,
however, remains unchanged.

From the integrand to scalar integrals. We now want to make contact
with the one-loop decomposition in terms of scalar integrals of Eq. (6.3). To
this end, notice that not every term appearing in Eqs. (6.155)–(6.159) sur-
vives loop integration. In particular, the l-dependent four-dimensional tensor
structures vanish upon performing the angular integration in the transverse
space.2

After integration, the amplitude can therefore be written in the simplified
form

IN =
∑

i1,i2,i3,i4,i5

ẽ
(0)
i1i2i3i4i5

Ii1i2i3i4i5

+
∑

i1,i2,i3,i4

d̃
(0)
i1i2i3i4

Ii1i2i3i4

+
∑

i1,i2,i3

c̃
(0)
i1i2i3

Ii1i2i3

+
∑
i1,i2

b̃
(0)
i1i2

Ii1i2 +
∑
i1

ã
(0)
i1
Ii1 + R.

(6.160)

Here Ii1...ir denote scalar loop integrals, while R contains the rational contri-
bution. Notice that the l-dependent structures vanish and a decomposition
of the form of Eq. (6.3), is precisely what remains.

2For example, in the four-point residue of Eq. (6.155), the terms proportional to d̃1(l·n4)

and d̃3(l · nϵ)
2(l · n4) vanish after integration, since they are odd under (l · n4) → −(l · n4).

In contrast, terms involving even powers of the extra-dimensional component (l ·nϵ) do not
generally vanish and can contribute to the rational part of the amplitude.
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The role of the D-dimensional loop momentum. Finally, we should
comment more of the role of the D-dimensional loop momentum to extract
the rational term contribution of an amplitude. We already hinted that the
rational term is precisely the reason why the dimensionality of the loop mo-
mentum must be treated carefully. Although the external kinematics can be
kept four-dimensional, the loop momentum entering the regularized integral
is genuinely D-dimensional. Its extra-dimensional component is represented
in the previous parametrizations by l · nϵ.

A calculation in which the loop momentum were restricted from the be-
ginning to four dimensions would set

l · nϵ = 0 (6.161)

and would therefore lose all information contained in structures such as

(l · nϵ)2, (l · nϵ)4, (l · nϵ)2(l · ni). (6.162)

These terms are invisible to strictly four-dimensional cuts, but can give non-
vanishing contributions after integration.

The origin of this effect can also be understood directly from PV reduction.
Taking [56]

D = 4− 2ϵ, (6.163)

the reduction coefficients may contain explicit dependence on ϵ. Rational
contributions arise when such terms multiply ultraviolet poles. Schematically,

Rational terms ∼ ϵB0(p;m
2
i ,m

2
j ), ϵA0(m

2
i ), (6.164)

since A0 andB0 are the ultraviolet-divergent scalar one-loop integrals. Indeed,

A0 ∼
m2

ϵ
+ O(ϵ0) B0 ∼

1

ϵ
+ O(ϵ0), (6.165)

so that

ϵ

(
1

ϵ
+ O(ϵ0)

)
= 1 + O(ϵ). (6.166)

Contributions of O(ϵ) can, when mutliplied with poles in 1/ϵ leave finite re-
mainders.

This explains why the rational term cannot, in general, be reconstructed
from a purely four-dimensional analysis. The missing information originates
from the D-dimensional structure of the loop momentum and of the reduction
coefficients. In the van Neerven–Vermaseren parametrization, this informa-
tion is encoded explicitly through the nϵ-dependent terms, which therefore
must be retained.



Chapter 7

Higgs production via gluon-fusion
at one-loop

In this section, we finally apply everything we have discussed so far to
the case of Higgs production via gluon fusion at one loop. This process is of
extreme importance in the panorama of particle physics. Indeed, it represents
the dominant Higgs production mechanism at the LHC and is therefore of
central importance for testing the Higgs boson properties.

Exploiting the spinor-helicity formalism discussed in Ch. 4, we were able
to determine tree-level scattering amplitudes from general principles such as
little-group scaling and locality. Furthermore, we specialized these tools to
the calculation of the gluon-fusion Higgs production process at tree level in
Ch. 5. The general principles we relied on provide a tree-level expression
that is not allowed in the SM, but which we were instead able to match onto
SMEFT.

The aim of this section is to find the one-loop BSM amplitude for gg → h.
In doing so, we will need to bring together not only the spinor-helicity formal-
ism, but also the characterization of one-loop amplitudes reported in Ch. 6.
In particular, both the decomposition into scalar integrals and generalized
unitarity methods will be implemented. Finally, we will provide a matching
onto the corresponding leading-order SMEFT amplitude of Eq. (3.19).

7.1 Extending the analysis to one loop

In the SM, Higgs production via gluon fusion is loop induced. Therefore,
if we want to extend the amplitude approach to one loop, we will need to re-
cover the SM result in our expression. Recovering the SM result then provides
a powerful benchmark for the calculation. Recall that in Sec. 5.1.1 we boot-
strapped the hgg amplitude at tree level. There, we obtained a non-vanishing
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h(p1)

ga(p2)

gb(p3)

k

k2

k3

+
h(p1)

gb(p3)

ga(p2)

k

k′2

k3

Figure 7.1: SM-like diagram contribution to Higgs production via gluon fusion.

contribution which already represents a beyond-the-Standard-Model (BSM)
contribution, which we report again here for completeness,

M
(
h, ga,+(p1), g

b,+(p2)
)
= δab

Chgg
5

Λ
[12]2. (7.1)

This refers to the case in which both gluons have positive helicity, while the
opposite-helicity configuration is reported in Eq. (5.18). Recall that these are
the only two non-vanishing helicity configurations, mixed gluon helicity lead
to vanishing amplitudes. After evaluating this amplitude, we matched it onto
SMEFT. This matching is possible because SMEFT contains specific higher-
dimensional operators that are able to generate a tree-level contribution to
the process of interest.

What happens at one-loop level? If we said that amplitude methods pro-
vide the model-independent contributions to a specific scattering process, why
do we need to extend the analysis even further? The main point is that loop
amplitudes contain more complicated non-analytic structures than in the tree-
level case. Actually, since hgg is a three-point scattering amplitude, it con-
tains no factorizable parts, namely, not even simple poles appear at tree level.
Conversely, once we go to loop level, we expect the amplitude to decompose
into a sum of scalar integrals, just as we saw in Eq. (6.3). Hence, divergences
may also appear.

Let us outline the strategy we want to pursue. The idea is to construct
the model-independent one-loop amplitude starting from the relevant model-
independent lower-point tree-level amplitudes entering the process. We have
already bootstrapped the relevant lower-point amplitudes for the one-loop
SM-like diagrams, namely Eqs. (5.25) and (5.52). These are the htt̄ and t̄tg
on-shell scattering amplitudes, respectively. They represent the basic building
blocks for the two diagrams of interest, reported in Fig. 7.1. We refer to these
diagrams as SM-like diagrams and assume that only the top quark flows in
the loop, since it is the heaviest quark and therefore gives the dominant
contribution. Notice that we are considering Higgs decay rather than Higgs
production. However, the two processes are related by crossing symmetry in
such a way that they are described by the same analytic amplitude. Hence, at
the amplitude level, there is no distinction between considering one process
or the other. Moreover, we use the same colors to denote the lower-point
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Higgs-top and top-gluon interactions as those used in Appendix A.2 for the
corresponding SMEFT vertices. However, here we use squared vertices to
indicate that we are employing the rules obtained via the amplitude method.

From a kinematic viewpoint, we are considering

h(p) → g(p2) + g(p3) (7.2)

where p is the incoming Higgs momentum, while p2 and p3 are the outgoing
momenta of the two external gluons. Therefore,

p2 = m2
h, p22 = p23 = 0, (7.3)

and momentum conservation implies

s = 2p2 · p3 = m2
h, 2p · p2 = m2

h, 2p · p3 = m2
h. (7.4)

Concerning the propagating internal particles, we call k the loop momen-
tum and define

k2 = k − p2, k′2 = k − p3, k3 = k − p2 − p3, (7.5)

as shown in the diagrams.

Now, let us consider the amplitude for the Higgs boson decay into two
positive-helicity gluons,

M++ =

∫
dDk

(2π)D
µ2ϵ I++(k). (7.6)

As already discussed in Sec. 5.1.1, the negative-helicity amplitude can be read-
ily obtained via a parity transformation. Assuming that the only diagrams
contributing to the process are the two reported above, we write

I++(k) =
A++(k)

d0d1d2
+

Ã++(k)

d0d1d3
. (7.7)

With the tilde notation, we denote the amplitude obtained by exchanging the
two gluons, namely

Ã++(k) = A++(k)
∣∣
p2↔p3

. (7.8)

The denominators d0, d1, d2, and d3 are defined as

d0 = k2 −m2, d1 = (k − p2 − p3)
2 −m2,

d2 = (k − p2)
2 −m2, d3 = (k − p3)

2 −m2,
(7.9)

where m denotes the top-quark mass. These are the denominators associated
with the internal propagators in the diagrams.

The aim of this section is therefore clear: to determine the explicit ex-
pression of M++ by exploiting amplitude methods, without referring to a
Lagrangian.
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In order to evaluate M++, we first compute the numerators of the inte-
grand, A++(k) and consequently Ã++(k). To approach this task, we first
sew together the three lower-point amplitudes entering the first diagram in
Eq. (7.1),

A++(k) = (−1) i3M
(
1h, (−k)ti,I , (k3)Lt̄ℓ

)
×M

(
k I
t̄i
, (−k2)tj ,J , (−2)a,+g

)
×M

(
(k2)

J
t̄j
, (−k3)tℓ,L, (−3)

b,+
g

)
= i δiℓ

(
cLLhtt̄⟨k

L
3 | −kI⟩+ cRR

htt̄ [k
L
3 | −kI ]

)
× (T a)ji

[
cgt̄t ε

+
µ (p2; p3)

(
⟨kI |γµ| −k2,J ] + ⟨−k2,J |γµ|kI ]

)
+ cRRR

gt̄t [kI | −2][−k2,J | −2]

]

× (T b)ℓj

[
cgt̄t ε

+
ν (p3; p2)

(
⟨kJ2 |γν | −k3,L] + ⟨−k3,L|γν |kJ2 ]

)
+ cRRR

gt̄t [kJ2 | −3][−k3,L| −3]

]
. (7.10)

The factor (−1) in the first line is inserted because of the fermion loop, while
i3 comes from taking into account the three propagators. Notice that we
choose the reference momenta of the two gluons to be r2 = p3 and r3 = p2.
Moreover, we assign the little-group indices I, J , and L to the massive top
quarks circulating in the loops. By employing the conventions for negative
momenta inside spinors given in Eq. (4.33), and using Tr[T aT b] = 1

2δ
ab to

evaluate the color factor of the diagram, we obtain

A++(k) = i
δab

2

(
−cLLhtt̄⟨k

L
3 |kI⟩+ cRR

htt̄ [k
L
3 |kI ]

)
×
[
cgt̄t ε

+
µ (p2; p3)

(
⟨kI |γµ|k2,J ]− ⟨k2,J |γµ|kI ]

)
+ cRRR

gt̄t [kI |2][k2,J |2]
]

×
[
cgt̄t ε

+
ν (p3; p2)

(
⟨kJ2 |γν |k3,L]− ⟨k3,L|γν |kJ2 ]

)
+ cRRR

gt̄t [kJ2 |3][k3,L|3]
]
,

(7.11)

where the polarizations vectors are defined in Eq. (4.60), and take the follow-
ing explicit form

ε+2,µ ≡ ε+µ (p2; p3) =
⟨3|γµ|2]√
2 ⟨32⟩

, ε+3,ν ≡ ε+ν (p3; p2) =
⟨2|γν |3]√
2 ⟨23⟩

. (7.12)
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They satisfy

ε2+,2 = ε2+,3 = 0, ε+,2 · ε+,3 =
[23]2

m2
h

. (7.13)

Moreover, the contractions with the external momenta always vanish,

pi · ϵj = 0, i, j = 2, 3. (7.14)

Now, we should multiply all terms together and perform some simplifi-
cations. These involve using much of the technology we introduced to deal
with both massless and massive spinors. The aim is to make the dependence
on the loop momentum k explicit. The reason for doing so will become clear
when performing the calculation explicitly.

Instead of evaluating A++(k) in its full form, it is convenient to first re-
cover the pure SM contribution and then evaluate the remaining BSM struc-
tures.

7.1.1 Obtaining the SM contribution

Let us consider the SM contribution to A++(k) in Eq. (7.11). To isolate
this contribution, we exploit the mapping of the model-independent coeffi-
cients onto the corresponding SM ones:

SM : cLLhtt̄ = cRR
htt̄ = −i yt√

2
, cgt̄t = −igs, cRRR

gt̄t = 0. (7.15)

This mapping was obtained in Ch. 5 when matching the htt̄ and t̄tg amplitudes
onto the SM. Recovering the pure SM contribution allows us to benchmark
the procedure and highlight the remaining BSM contribution.

Upon using the SM couplings, Eq. (7.11) reduces to a much simpler ex-
pression,

ASM
++(k) = − 2παsm

v
δab
(
[kL3 |kI ]− ⟨kL3 |kI⟩

)
× ε+µ (p2; p3)

(
⟨kI |γµ|k2,J ]− ⟨k2,J |γµ|kI ]

)
× ε+ν (p3; p2)

(
⟨kJ2 |γν |k3,L]− ⟨k3,L|γν |kJ2 ]

)
. (7.16)

where, in place of the Yukawa coupling we used

yt =

√
2m

v
, (7.17)

with v the vacuum expectation value of the Higgs boson, measured to be
v ≃ 246Gev [2]. Moreover, we use the strong coupling constant αs = g2s/(4π).

The expression above contains eight different terms we need to evaluate.
The explicit computation is reported in Appendix D.1.1. We end up with the
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following expression

ASM
++(k) = − 2παsm

v
δabε+µ (p2; p3) ε

+
ν (p3; p2)

×

{
m

[
Tr
(
σ̄ασν σ̄βσµ

)
+Tr

(
σασ̄νσβσ̄µ

)]
(k3,αk2,β + kαk2,β)

+m

[
Tr
(
σ̄ασβσ̄νσµ

)
+Tr

(
σασ̄βσν σ̄µ

)]
kαk3,β

+m3

[
Tr (σ̄νσµ) + Tr (σν σ̄µ)

]}
. (7.18)

Notice that we have managed to achieve what was stated above, namely
to isolate the dependence on the loop momentum k. To proceed further,
we should evaluate the trace using Eqs. (B.36) and (B.37). This step was
automated using Form [57–59]. Moreover, exploiting the kinematic relations
in Eqs. (7.3) and (7.4), we obtain

ASM
++(k) = −8παsm

2

v
δab

{
2 (p2 · k)

(
ε+2 · ε+3

)
+
(
ε+2 · ε+3

) (
m2 − k2

)
+ 4

(
k · ε+2

) (
k · ε+3

)
−
(
ε+2 · ε+3

) m2
h

2

}
, (7.19)

where we implemented the orthogonality of the polarization vectors to the
physical space, Eq. (7.14).

At this point, we can convert this expression back to the spinor-helicity
formalism. The reason for doing so is that the spinor-helicity formalism allows
for a more direct implementation of generalized unitarity cuts, as we will see
later. In doing so, we must take care when treating the loop momentum k. In
particular, we always want it to be placed inside spinor bilinear forms. Doing
so, ensures the correct implementation of the upcoming generalized unitarity
algorithm. To perform the conversion, we need Eq. (4.39) to reconstruct the
massless momenta in terms of spinors, Eq. (7.12) for the explicit expressions
of the polarization vectors, and their dot product in Eq. (7.13). We also
implement the following spinor relation

⟨23⟩⟨32⟩ [23]
2

[23]2
= −⟨23⟩[32]⟨32⟩[23] 1

[23]2
= −

m4
h

[23]2
, (7.20)

which allows to collect a common − [23]2

m2
h

factor in front of the amplitude. We

are eventually left with
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ASM
++(k) = − 8παsm

2

v
δab
(
− [23]2

m2
h

){
− ⟨2|/k|2]−

(
m2 − k2

)
+
m2

h

2

+
2

m2
h

[2|/k|3⟩[3|/k|2⟩

}
.

(7.21)

Without having to translate back to spinor variables, we could have imple-
mented the explicit expressions of the polarization vectors in Eq. (7.16) from
the outset. In this way, we would have also bypassed the evaluation of the
traces. In Appendix D.1.2, we show this alternative way of performing the
present calculation, in which the slashed polarization vectors are made explicit
from the outset. This method, however, obscures the last term appearing in
Eq. (7.21), which can still be recovered by exploiting the Schouten identity.
Though still not evident here, the form obtained after applying the Schouten
identity allows for the determination of the rational-term contributions, which
would not otherwise emerge from the original form. Therefore, this point re-
quires some care and is of physical importance.

Finally, we can straightforwardly obtain the expression for the numerator
Ã++(k), in which the two gluon momenta are exchanged. Equation (7.8)
yields

Ã SM
++(k) = − 8παsm

2

v
δab
(
− [32]2

m2
h

){
− ⟨3|/k|3]−

(
m2 − k2

)
+
m2

h

2

+
2

m2
h

[3|/k|2⟩[2|/k|3⟩

}
.

(7.22)
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7.2 Implementation of a generalized uni-
tarity algorithm

In this section, we make use of the techniques discussed in Ch. 6, namely
generalized unitarity and the van Neerven–Vermaseren basis. The goal is to
derive the expression for M++ reported in Eq. (7.6). We momentarily pause
the SM derivation, since what we discuss here does not require specifying a
particular theory and will also be used for the BSM terms.

Let us start by considering the following expansion in terms of scalar
integrals,

S = c012
1

2

3

0

1

2 + c013
1

3

2

0

1

3

+ b01
1

2

3

0

1
+ b02

2

1

3

0

2
+ b03

3

1

2

0

3

+ b12
3

1

2

2

1
+ b13

2

1

3

3

1

+ a0
1

2

3

0

+ a1
1

2

3

1

+ a2
1

2

3

2

+ a3
1

2

3

3

+

+ R,
(7.23)

where R is the rational term. The scalar triangle, bubble, and tadpole dia-
grams are defined as follows
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A0[1] ≡
i

=

∫
dDk

(2π)D
µ2ϵ

di
. (7.24)

B0[1] ≡
i

j
=

∫
dDk

(2π)D
µ2ϵ

di dj
. (7.25)

C0[1] ≡
i

j

l =

∫
dDk

(2π)D
µ2ϵ

di dj dl
, (7.26)

where di, with i ∈ {0, 1, 2, 3}, are defined in Eq. (7.9), and the arguments of
the square brackets denote the numerator of the integral. With respect to the
definitions provided in Eqs. (6.4), (6.5), and (6.6), we allow for the presence of
a numerator, denoted within the square brackets, which in this case is simply
1. Moreover, due to the equal masses of the internal propagators, all tadpole
integrals are equal, as are the two triangle integrals, up to a redefinition of the
loop momentum. The bubble integrals instead fall into two distinct classes,
according to the invariant momentum flowing through them. Nevertheless,
we retain all of them, since they make explicit which propagators can be cut.
From now on, we label the propagators appearing in the above diagrams by
the corresponding index i ∈ {0, 1, 2, 3}.

We use the above expansion as an ansatz for the structure of the amplitude
of interest, M:

1

2

3

0

1

2 + 1

3

2

0

1

3 = S. (7.27)

This equation sets the aim of this section, namely to reconstruct the am-
plitude M by determining the explicit expressions for the coefficients of S.
Notice that we do not specify the helicities of the gluons in M, since this
procedure applies to any gluon-helicity configuration.

To exploit generalized unitarity methods for this reconstruction, we need
two main ingredients: the cutting procedure discussed in Sec. 6.3 and a suit-
able D-dimensional parametrization of the loop momentum. Before outlin-
ing the reconstruction algorithm, we therefore specialize the van Neerven–
Vermaseren basis introduced in Sec. 6.3.1 to the present process.

Van Neerven–Vermaseren parametrization of the loop momentum.
In Ch. 6 we explained what a van Neerven–Vermaseren basis is, and discussed
its applicability in the context of generalized unitarity. Now, we need to apply
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the previous construction to the process of interest. What we want to obtain
is an expansion of the loop momentum similar to the one of Eq. (6.154).

We defined the kinematics of the process in Eq. (7.2), hence from momen-
tum conservation p1 = p2 + p3. This implies that only two external momenta
are linearly independent. Hence, for the triangle topology contributing to
the hgg amplitude, the four-dimensional physical space is two-dimensional,
namely

DP = 2, (7.28)

where Eq. (6.92) was used. The corresponding van Neerven–Vermaseren dual
vectors can be found by specializing Eq. (6.99) to the above kinematics:

vµ1 =
pµ3

p2 · p3
, vµ2 =

pµ2
p2 · p3

, (7.29)

so that

v1 · p2 = 1, v1 · p3 = 0, v2 · p2 = 0, v2 · p3 = 1. (7.30)

The two remaining four-dimensional directions that parametrize the trans-
verse space, can be conveniently chosen in terms of the polarization vectors
of the external gluons. For positive helicities polarization vectors we choose
the ones defined in Eq. (7.12), where we chose the momentum of the other
gluon as reference momentum

With this choice of reference momenta, both polarization vectors are or-
thogonal to the entire physical space,

pi · ϵj = 0, i, j = 2, 3. (7.31)

Thus, εµ+,2 and εµ+,3 provide a null basis for the two-dimensional transverse
space associated with the hgg kinematics.

A D-dimensional loop momentum can consequently be decomposed as

kµ = a pµ2 + b pµ3 + c εµ+,2 + d εµ+,3 + kϵ n
µ
ϵ , (7.32)

where nµϵ parametrizes the extra-dimensional component of the loop momen-
tum. The decomposition therefore separates naturally into

a pµ2 + b pµ3︸ ︷︷ ︸
physical space

+ c εµ+,2 + d εµ+,3︸ ︷︷ ︸
transverse space

+ kϵ n
µ
ϵ︸ ︷︷ ︸

extra-dimensional space

. (7.33)

This is the explicit realization of the van Neerven–Vermaseren decompo-
sition for the hgg kinematics. The projections along p2 and p3 are reducible
scalar products and can be expressed in terms of differences of inverse prop-
agators. On the other hand, the projections along ε+,2 and ε+,3 represent
the irreducible four-dimensional transverse components of the loop momen-
tum. Finally, the component proportional to nµε contains the genuinely D-
dimensional information and becomes essential for reconstructing the rational
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part of the one-loop amplitude. The coefficients a, b, c, and d are initially free
and therefore parametrize a generic loop momentum. The unitarity cuts will
constrain these coefficients by imposing the appropriate on-shell conditions
on the internal propagators.

Algorithm implementation. With the van Neerven–Vermaseren parametriza-
tion at hand, the generalized-unitarity reconstruction can be summarized as
follows:

1. We perform unitarity cuts on both sides of Eq. (7.27), starting from
the highest number of internal propagators that can be simultaneously
cut. By performing triple cuts, we obtain the coefficients c012 and c013;
cutting two propagators instead allows us to single out the contributions
of b01, b02, b03, b12, and b13, after subtracting the already determined
higher-topology contributions; finally, single cuts allow us to evaluate
a0, a1, a2, and a3.

2. Once the diagrams are cut, we are left with a set of equations involving
only cut diagrams. More precisely, when we perform a cut through an
internal propagator, we put the corresponding particle on shell, meaning
that we replace the propagator 1/di with the Dirac delta distribution
−2πi δ(di), as prescribed by the cutting rule in Eq. (6.44). It is therefore
convenient to introduce the notation

Cuti1···in [M] ≡ M| 1
dir

→(−2πi)δ(dir ), r=1,...,n . (7.34)

The set of equations involving cut diagrams is then obtained by cutting
both sides of Eq. (7.27),

Cuti1···in [M] = Cuti1···in [S] . (7.35)

For instance, for the first triple cut, the above equation reduces to

Cut012 [M] = c012

∫
dDk

(2π)D
µ2ϵ (−2πi)3δ(d0)δ(d1)δ(d2), (7.36)

since, on the S side, only the first scalar triangle survives when prop-
agators 0, 1, and 2 are simultaneously put on shell. Conversely, the
left-hand side reads

Cut012 [M] =

∫
dDk

(2π)D
µ2ϵA(k) (−2πi)3δ(d0)δ(d1)δ(d2), (7.37)

where A(k) denotes the corresponding numerator.
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3. For each cut, we constrain the loop-momentum parametrization of Eq. (7.32)
by imposing the appropriate on-shell conditions,

di1(k) = di2(k) = . . . = din(k) = 0. (7.38)

These conditions imply that the parameters a, b, c, and d are no longer
all independent and therefore determine the corresponding on-shell parametriza-
tion of the loop momentum for each cut. In Sec. D.2, we explain this
procedure in more detail, collecting the resulting parametrizations for
all the cuts in Tab. D.1.

4. Once the constrained loop momentum has been obtained, it is substi-
tuted into the corresponding numerator A(k). The coefficient associated
with the cut can then be extracted by comparing the two sides of the
cut equation, since the remaining cut measure is identical on both sides.
For instance, for the triple cut 012, in the present case one obtains

c012 = A(k)|d0=d1=d2=0 . (7.39)

The same procedure is applied recursively to lower topologies, after
subtracting the contributions associated with the coefficients already
determined from higher cuts.

Moreover, since the loop momentum is parametrized in D = 4− 2ϵ di-
mensions, the cut solutions retain the dependence on the extra-dimensional
component kϵ. Terms proportional to k2ϵ contain the genuinely D-
dimensional information and give rise, after integration, to the rational
contribution R.

The algorithm described above was implemented in Mathematica [26]
using the package SMaSH [27]. This package provides a convenient frame-
work for manipulating both massless and massive spinor-helicity variables,
making it particularly suitable for the process under consideration.

For the SM amplitude, the calculation was first carried out analytically by
hand and subsequently reproduced using the implementation described above.
The agreement between the two calculations provides a non-trivial benchmark
for the algorithm before applying it to the more general amplitude.

7.3 SM amplitude

Having set up the algorithm for extracting the coefficients of the scalar-
integral decomposition in Eq. (7.23), we can reconstruct the SM amplitude.
In Tab. 7.1, we report the expressions obtained for the triangle, bubble, and
tadpole scalar coefficients. Notice that both the bubble and tadpole coeffi-
cients sum to zero, as expected, since the SM amplitude must be divergence
free. As an example, in Appendix D.3, we provide a detailed derivation of the
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coefficient b01 by exploiting the algorithm described in the previous section.

Let us now reconstruct the amplitude for the hgg process in the SM. To
this end, we combine the scalar-integral decomposition with the expressions
for the coefficients obtained through the generalized unitarity algorithm. We
obtain

MSM
++ = −8παsm

2

v
δab
(
− [23]2

m2
h

)
2×

{
C0

(
−2m2 +

m2
h

2

)
− i

16π2

}
, (7.40)

where the two triangle scalar integrals were cast into a single C0(p2, p3;m
2,m2,m2)

through loop-momentum redefinitions. We pause briefly to discuss the rational-
term contribution. Computationally, its contribution, reported in the last row
of Tab. 7.1, comes from performing the triple cuts 012 and 013. This means
that, to extract the actual value of R, we need to evaluate [15]

R = −δab
(
− [23]2

m2
h

)
32πm2αs

v
C0[k

2
ϵ ] = δab

(
− [23]2

m2
h

)
iαsm

2

πv
, (7.41)

in the notation introduced in Eq. (7.26). This is precisely the contribution in
MSM

++.
Now, we can exploit the following relation [60]

C0(p2, p3;m
2,m2,m2) =

∫
dDk

(2π)D
µ2ϵ

(k2 −m2)[(k − p2)2 −m2][(k + p3)2 −m2]

= − i

16π2
2

m2
h

f(τ),

(7.42)

with τ ≡ 4m2

m2
h

and f(τ) defined in Eq. (A.28). Then, the above amplitude

reads

MSM
++ = i

αs

3πv
δab
(
− [23]2

m2
h

)
m2

h

2
F1(τ). (7.43)

This result agrees with the amplitude computed in Eq. (3.19). To see this
explicitly we first set to zero all the SMEFT Wilson coefficients, then we
exploit Eqs. (7.13), (7.14) and (7.4) to perform the kinematic contractions
in the spinor-helicity formalism. The all-negative-helicity amplitude can be
simply obtained via a parity transformation,

MSM
−− = i

αs

3πv
δab
(
−⟨23⟩2

m2
h

)
m2

h

2
F1(τ). (7.44)

Here, we have introduced the standard form factor

F1(τ) =
3

2
τ [1 + (1− τ) f(τ)] . (7.45)
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c012 c013

Triple cut
4πm2αs

v

(
4m2 −m2

h

) 4πm2αs

v

(
4m2 −m2

h

)

b01 b02 b03 b12 b13

Bubble 0 0 0 0 0

a0 a1 a2 a3

Tadpole −16πm2αs

vm2
h

−16πm2αs

vm2
h

16πm2αs

vm2
h

16πm2αs

vm2
h

R012 R013

Rational −16πm2αs

v
k2ϵ −16πm2αs

v
k2ϵ

Table 7.1: Triple-cut, bubble, tadpole, and rational coefficients. The common factor
δab
(
−[23]2/m2

h

)
has been factored out from all coefficients. The terms proportional

to k2ϵ have been separated from the triple-cut coefficients and collected in the rational
contribution. They will lead to the rational term only once integrated.

Although the two amplitudes are not identical, since they carry opposite
little-group weights, they are characterized by the same scalar form factor.
Indeed, parity exchanges angle and square brackets, ⟨23⟩ ↔ [23], while leaving
the scalar coefficient unchanged. Therefore, in the SM, the ++ and −−
helicity configurations contain the same dynamical information, while the
factors

(
−[23]2/m2

h

)
and

(
−⟨23⟩2/m2

h

)
only encode their different helicity

structures.
For real external momenta, the two spinor structures are related by com-

plex conjugation. Using the property reported in Eq. (4.20), one finds(
[23]2

m2
h

)(
[23]2

m2
h

)∗
=

[23]2⟨32⟩2

m4
h

=

(
[23]⟨32⟩
m2

h

)2

= 1. (7.46)

Hence, these helicity-dependent factors drop out from the squared amplitude,
and therefore ∣∣MSM

++

∣∣2 = ∣∣MSM
−−
∣∣2 . (7.47)
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7.4 BSM amplitude at LO

In the previous section, we computed the SM amplitude for Higgs pro-
duction via gluon fusion. We were able to set the notation and establish
the method for recovering the well-known SM result. Indeed, it served as a
benchmark for the algorithm based on generalized unitarity.

In this section, we instead focus on all possible BSM structures that can
emerge at LO in the Λ expansion from the same SM-like diagrams reported
in Eq. (7.1). Recall that, before specializing the amplitude to the SM case,
we obtained the general expression for the first diagram, namely Eq. (7.11),
which we report again here for completeness:

A++(k) = i
δab

2

(
−cLLhtt̄⟨k

L
3 |kI⟩+ cRR

htt̄ [k
L
3 |kI ]

)
×
[
cgt̄t ε

+
µ (p2; p3)

(
⟨kI |γµ|k2,J ]− ⟨k2,J |γµ|kI ]

)
+ cRRR

gt̄t [kI |2][k2,J |2]
]

×
[
cgt̄t ε

+
ν (p3; p2)

(
⟨kJ2 |γν |k3,L]− ⟨k3,L|γν |kJ2 ]

)
+ cRRR

gt̄t [kJ2 |3][k3,L|3]
]
,

(7.48)

This expression was obtained by sewing together the tree-level amplitudes
for positive-helicity gluons. The amplitude for the second SM-like diagram,
which we denote by Ã++(k), can then be obtained by exchanging the two
gluon momenta.

Since we have already computed the SM contribution to this amplitude,
we can rewrite A++(k) in a form that makes the SM and BSM structures
explicit,

A++(k) = i
δab

2

[
cRR
htt̄ + cLLhtt̄

2

(
−⟨kL3 |kI⟩+ [kL3 |kI ]

)
+
cRR
htt̄ − cLLhtt̄

2

(
⟨kL3 |kI⟩+ [kL3 |kI ]

) ]
×
[
cgt̄t ε

+
µ (p2; p3)

(
⟨kI |γµ|k2,J ]− ⟨k2,J |γµ|kI ]

)
+ cRRR

gt̄t [kI |2][k2,J |2]
]

×
[
cgt̄t ε

+
ν (p3; p2)

(
⟨kJ2 |γν |k3,L]− ⟨k3,L|γν |kJ2 ]

)
+ cRRR

gt̄t [kJ2 |3][k3,L|3]
]
,

(7.49)

where the first two lines now resemble the parametrization of the ht̄t ampli-
tude reported in Eq. (5.30). In particular, the piece proportional to (cRR

htt̄ − cLLhtt̄)/2
is responsible for a parity-violating interaction between the Higgs and the top
quarks. Conversely, (cRR

htt̄ + cLLhtt̄)/2 contains the SM coupling and, at most,
modifications to the Yukawa coupling.

Similarly to before, we now need to perform the spinor contractions. We
can recycle much of the calculation performed in the previous section, except
for the terms involving the coefficient cRRR

gt̄t . For convenience, we display these
two parts separately.
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7.4.1 Computation of the SM-like numerator

Let us consider the SM-like term contained in Eq. (7.48). In practice, we
neglect the coefficient cRRR

gt̄t and consider it only later. Hence,

ASM-like
++ (k) = i

δab

2

(
cRR
htt̄ [k

L
3 |kI ]− cLLhtt̄⟨k

L
3 |kI⟩

)
× cgt̄t ε

+
µ (p2; p3)

(
⟨kI |γµ|k2,J ]− ⟨k2,J |γµ|kI ]

)
× cgt̄t ε

+
ν (p3; p2)

(
⟨kJ2 |γν |k3,L]− ⟨k3,L|γν |kJ2 ]

)
, (7.50)

where in the first line we factored out a minus sign. The above contribution
resembles the pure SM one of Eq. (7.16), except for the use of general coeffi-
cients instead of the corresponding SM ones. For this reason, the calculation
is essentially the same and is reported explicitly in Appendix D.1. We obtain

ASM-like
++ (k) = i

δab

2
c2gt̄t ε

+
µ (p2; p3) ε

+
ν (p3; p2)

×

{
m

[
cRR
htt̄ Tr

(
σ̄ασν σ̄βσµ

)
+ cLLhtt̄ Tr

(
σασ̄νσβσ̄µ

)]
k3,αk2,β

+m

[
cLLhtt̄ Tr

(
σ̄ασν σ̄βσµ

)
+ cRR

htt̄ Tr
(
σασ̄νσβσ̄µ

)]
kαk2,β

+m

[
cRR
htt̄ Tr

(
σ̄ασβσ̄νσµ

)
+ cLLhtt̄ Tr

(
σασ̄βσν σ̄µ

)]
kαk3,β

+m3

[
cRR
htt̄ Tr (σ̄

νσµ) + cLLhtt̄ Tr (σ
ν σ̄µ)

]}
. (7.51)

Using Eqs. (B.36), (B.38) and (B.39), the amplitude can be rearranged as

ASM-like
++ (k) = i

c2gt̄tm

2
δab ε+µ (p2; p3) ε

+
ν (p3; p2)

{
cRR
htt̄ + cLLhtt̄

2

[
Tr
(
γαγνγβγµ

)
(k3,αk2,β + kαk2,β)

+ Tr
(
γαγβγνγµ

)
kαk3,β +m2Tr (γµγν)

]

+
cRR
htt̄ − cLLhtt̄

2
4i ϵανβµ

(
− k3,αk2,β + kαk2,β − kαk3,β

)}
.

(7.52)

Notice that (cRR
htt̄ + cLLhtt̄)/2 multiplies the same contribution obtained in the

SM case of Eq. (7.18), whereas the other combination is responsible for parity
violation. These behaviors were expected.
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To proceed further, we need to evaluate the traces and contract the indices.
We have already done this for the SM part, obtaining Eq. (7.21). On the other
hand, for the epsilon-dependent term in the above equation, we implement
the momentum definitions in Eq. (7.5), together with Eq. (B.43). Eventually,
the expression reads

ASM-like
++ (k) = i 2 c2gt̄tmδab

(
− [23]2

m2
h

){
cRR
htt̄ + cLLhtt̄

2

[
− ⟨2|/k|2]−

(
m2 − k2

)
+
m2

h

2
+

2

m2
h

[2|/k|3⟩[3|/k|2⟩

]
+
cRR
htt̄ − cLLhtt̄

2

[
−
m2

h

2

]}
.

(7.53)
As a crosscheck, notice that by using the SM couplings in Eq. (7.15), the
above equation correctly reduces to Eq. (7.21).

7.4.2 Computation of the pure BSM factor

Let us now consider the left over pieces, namely the ones proportional to
the coefficient cRRR

gt̄t . These terms are purely BSM. Their contribution can be

extracted from Eq. (7.48), and read

A
cRRR
gt̄t

++ (k) = i
δab

2
cgt̄t c

RRR
gt̄t

(
−cLLhtt̄⟨k

L
3 |kI⟩+ cRR

htt̄ [k
L
3 |kI ]

)
×

{
ε+µ (p2; p3)

(
⟨kI |γµ|k2,J ]− ⟨k2,J |γµ|kI ]

)
[kJ2 |3][k3,L|3]

+ [kI |2][k2,J |2] ε+ν (p3; p2)
(
⟨kJ2 |γν |k3,L]− ⟨k3,L|γν |kJ2 ]

)}
.

(7.54)

Since we are interested in the leading-order amplitude in the 1/Λ expansion,
we must retain only the contributions linear in the coupling cRRR

gt̄t . This is
because, as already discussed in Sec. 5.1.3, dimensional analysis suggests the
presence of a dimension-6 operator generating this coupling.

To perform the calculation, we first need to rewrite the two new terms in
a more convenient form. This is because both [kJ2 |3][k3,L|3] and [kI |2][k2,J |2]
obscure the presence of a polarization vector that can be factored out:

[kJ2 |3] [k3,L|3] =
1

2
√
2
ε+3,ν

(
[kJ2 |3] ⟨3|γν |k3,L] + [k3,L|3] ⟨3|γν |kJ2 ]

)
. (7.55)

[kI |2] [k2,J |2] =
1

2
√
2
ε+2,µ

(
[kI |2] ⟨2|γµ|k2,J ] + [k2,J |2] ⟨2|γµ|kI ]

)
. (7.56)

These can be straightforwardly verified by using the explicit expressions of
the slashed polarization vectors of Eq. (4.63).
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Using Eqs. (7.55) and (7.56), we can factor out the two polarization vectors
ε+2,µ and ε+3,ν to ease the computation; obtaining

A
cRRR
gt̄t

++ (k) = − i
δab

2
cgt̄t c

RRR
gt̄t

1

2
√
2
ε+2,µ ε

+
3,ν

(
cLLhtt̄⟨k

L
3 |kI⟩ − cRR

htt̄ [k
L
3 |kI ]

)
×

{(
⟨kI |γµ|k2,J ]− ⟨k2,J |γµ|kI ]

)
×
(
[kJ2 |3] ⟨3|γν |k3,L] + [k3,L|3] ⟨3|γν |kJ2 ]

)
+
(
[kI |2] ⟨2|γµ|k2,J ] + [k2,J |2] ⟨2|γµ|kI ]

)
×
(
⟨kJ2 |γν |k3,L]− ⟨k3,L|γν |kJ2 ]

)}
. (7.57)

where we collected a minus sign in the first line. In Appendix D.4, we ex-
plicitly show all the steps involved in performing the spinor contractions.
Eventually, we convert the amplitude back to the spinor-helicity formalism
by exploiting Eqs. (4.39), (7.12), and (7.20). We obtain the following result:

A
cRRR
gt̄t

++ (k) = i
cgt̄t c

RRR
gt̄t

2
√
2

δab
(
− [23]2

m2
h

){
m2m2

h c
RR
htt̄

+ cLLhtt̄

[
− ⟨2|/k|2] [3|/k|3⟩+ ⟨2|/k|2]

(
k2 −m2

)
− ⟨2|/k|2]2 + k2m2

h + ⟨2|/k|3] ⟨3|/k|2]

]}
.

(7.58)

An important point is that this amplitude was obtained by setting to zero all
γ5 terms appearing in the traces, as highlighted in Eq. (D.66) This corresponds
to obtain the CP-conserving part of the amplitude only. In other words,
we adopt the NDR-Discard prescription [61], in which the remaining γ5-
odd traces are set to zero. We did the same for the SMEFT amplitude of
Eq. (3.19).

7.4.3 Complete amplitude

We can now combine the SM-like contribution with the term linear in
cRRR
gt̄t . Since both contributions share the same overall kinematic factor, it is
convenient to factor it out and write the complete numerator, up to linear
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order in cRRR
gt̄t , in a single expression:

A++(k) = i cgt̄t δ
ab

(
− [23]2

m2
h

){
2 cgt̄tm

[
cRR
htt̄ + cLLhtt̄

2

(
− ⟨2|/k|2]−

(
m2 − k2

)
+
m2

h

2
+

2

m2
h

[2|/k|3⟩[3|/k|2⟩

)
+
cRR
htt̄ − cLLhtt̄

2

(
−
m2

h

2

)]

+
cRRR
gt̄t

2
√
2

[
m2m2

h c
RR
htt̄ + cLLhtt̄

(
− ⟨2|/k|2] [3|/k|3⟩+ ⟨2|/k|2]

(
k2 −m2

)
− ⟨2|/k|2]2 + k2m2

h + ⟨2|/k|3] ⟨3|/k|2]

)]}
.

(7.59)
The next step is to reconstruct the full amplitude. To this end, we employ
the generalized unitarity algorithm described in Sec. 7.2. This calculation
was performed completely automatically using Mathematica and its inter-
face with SMaSH. In Tab. 7.2, we collect the expressions for the coefficients
obtained. Notice that, upon using the SM couplings defined in Eq. (7.15), the
BSM coefficients reduce to the corresponding SM ones reported in Tab. 7.1.

Let us now provide the full expression for the reconstructed amplitude. In-
serting the coefficients of Tab. 7.2 into the amplitude expansion of Eq. (7.32),
we obtain

M++ = δab
(
− [23]2

m2
h

){
2C0

[
im2m2

h cgt̄t c
RRR
gt̄t cRR

htt̄

2
√
2

+ im c 2gt̄t
(
cLLhtt̄ + cRR

htt̄

)(m2
h

2
− 2m2

)
+
i

2
mc 2gt̄tm

2
h

(
cLLhtt̄ − cRR

htt̄

) ]

+B0

i cgt̄tm
2
h c

RRR
gt̄t cLLhtt̄

2
√
2

− i

16π2

[
i cgt̄tm

2
h c

RRR
gt̄t cLLhtt̄

2
√
2

+ 2im c 2gt̄t
(
cLLhtt̄ + cRR

htt̄

) ]}
.

(7.60)

where C0 and B0 indicate C0

(
p2, p3;m

2,m2,m2
)
and B0

(
p1;m

2,m2
)
, respec-

tively. We stress that the above expression is not the full LO result of the
h→ gg process. This is because, as already stated, we are taking into account
the SM-like diagrams of Fig. 7.1 only. A complete expression should contain
also the terms obtained from sewing four-point vertices which would appear
by considering diagrams (6) and (7) of Fig. A.1.
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c012 c013

Triple cut

im2m2
h cgt̄t c

RRR
gt̄t cRR

htt̄

2
√
2

+ im c 2gt̄t
(
cLLhtt̄ + cRR

htt̄

)
×
(
m2

h

2
− 2m2

)
+
i

2
mc 2gt̄tm

2
h

(
cLLhtt̄ − cRR

htt̄

)

im2m2
h cgt̄t c

RRR
gt̄t cRR

htt̄

2
√
2

+ im c 2gt̄t
(
cLLhtt̄ + cRR

htt̄

)
×
(
m2

h

2
− 2m2

)
+
i

2
mc 2gt̄tm

2
h

(
cLLhtt̄ − cRR

htt̄

)

b01 b02 b03 b12 b13

Bubble
i cgt̄tm

2
h c

RRR
gt̄t cLLhtt̄

2
√
2

0 0 0 0

a0 a1

Tadpole
i

4
cgt̄t

(
8mcgt̄t
m2

h

(
cLLhtt̄ + cRR

htt̄

)
−

√
2(x+ y)

x+ y − 1
cRRR
gt̄t cLLhtt̄

)
i

4
cgt̄t

(
8mcgt̄t
m2

h

(
cLLhtt̄ + cRR

htt̄

)
+

√
2(x+ y)

x+ y − 1
cRRR
gt̄t cLLhtt̄

)

a2 a3

Tadpole −
2im c 2gt̄t

(
cLLhtt̄ + cRR

htt̄

)
m2

h

−
2im c 2gt̄t

(
cLLhtt̄ + cRR

htt̄

)
m2

h

R012 R013

Rational

i cgt̄tm
2
h k

2
ϵ c

RRR
gt̄t cLLhtt̄

2
√
2

+ 2imk2ϵ c
2
gt̄t

(
cLLhtt̄ + cRR

htt̄

)
i cgt̄tm

2
h k

2
ϵ c

RRR
gt̄t cLLhtt̄

2
√
2

+ 2imk2ϵ c
2
gt̄t

(
cLLhtt̄ + cRR

htt̄

)
Table 7.2: Triple-cut, bubble, tadpole, and rational coefficients. The common factor
δab
(
−[23]2/m2

h

)
has been omitted from all coefficients for brevity. The coefficients

associated with the cuts (012) and (013) are identical for both the triple-cut and
rational contributions. They will lead to the rational term only once integrated.
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7.4.4 Matching onto SMEFT

In this section, we provide the matching onto SMEFT of the amplitude for
Higgs production via gluon fusion obtained in Eq. (7.60). The complete LO
SMEFT amplitude is reported in Eq. (A.25). However, here we focus only
on the SM-like contributions, namely on diagrams (2), (3), (4), and (5) of
Fig. A.1. Hence, we neglect both the CφG contribution, which arises from the
tree-level diagram, and the term proportional to B0(0;m

2,m2), which comes
from the last two diagrams of Fig. A.1.

We also take into account another modification with respect to Eq. (A.25).
In order to find the correct expressions for the coefficients cLLhtt̄ and c

RR
htt̄ , we re-

tain the CP-odd contribution to the Higgs-top interaction, namely Eq. (A.18).
This means taking into account the presence of γ5, which multiplies the imag-
inary part of C33

uφ. To this end, we cannot employ the NDR-Discard pre-
scription for evaluating the Dirac traces, as discussed in Sec. A.2.1. Instead,
we make use of the BMHV scheme [62, 63]. Concerning the top-gluon inter-
actions, we instead retain only the CP-even part.

Applying these modifications, the SMEFT amplitude of the SM-like dia-
grams of Fig. 7.1 only, can be written as

MSMEFT
++ = − m[23]2

Λ2
δab

{
8παs

m2
hv

X

[(
4m2 −m2

h

)
C0 +

i

8π2

]
− 4i

√
2παsv

2 ImC33
uφC0

+ 4
√
2παs ReC33

uG

[(
B0 −

i

16π2

)
+ 2m2C0

]}
,

(7.61)
where X is defined in Eq. (A.26), yet we report it here for completeness

X = Cφ□mv
2 − 1

4
CφDmv

2 − 1√
2
Re
(
C33
uφ

)
v3 + Λ2m. (7.62)

We can now compare Eq. (7.61) with the corresponding amplitude obtained
from the on-shell construction. The latter can be written as

M++ = − [23]2δab

{
8iπαsm

m2
h

(
cLLht̄t + cRR

ht̄t

2

)[(
4m2 −m2

h

)
C0 +

i

8π2

]

− 8iπαsm

(
cLLht̄t − cRR

ht̄t

2

)
C0

+

√
παs√
2

cRRR
gt̄t

[
cLLht̄t

(
B0 −

i

16π2

)
+ 2m2cRR

ht̄t C0

]}
,

(7.63)
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where cgt̄t = −2i
√
παs was used. We can now match Eqs. (7.61) and (7.63).

First, matching the parity-even contribution gives

i

(
cLLht̄t + cRR

ht̄t

2

)
=

X

Λ2v
. (7.64)

The contribution proportional to ImC33
uφ instead fixes the parity-odd com-

bination,

i

(
cLLht̄t − cRR

ht̄t

2

)
=

iv2√
2Λ2

ImC33
uφ. (7.65)

Combining these two relations and using the definition of X, the two co-
efficients are independently fixed as

i cLLht̄t =
m

v
+
mv

Λ2

(
Cφ□ − 1

4
CφD

)
− v2√

2Λ2
ReC33

uφ +
iv2√
2Λ2

ImC33
uφ,

i cRR
ht̄t =

m

v
+
mv

Λ2

(
Cφ□ − 1

4
CφD

)
− v2√

2Λ2
ReC33

uφ − iv2√
2Λ2

ImC33
uφ.

(7.66)
Finally, the terms proportional to ReC33

uG give

cRRR
gt̄t cLLht̄t =

8m

Λ2
ReC33

uG, (7.67)

cRRR
gt̄t cRR

ht̄t =
8m

Λ2
ReC33

uG. (7.68)

Since cRRR
gt̄t starts at O(Λ−2), only the SM part of cLLht̄t and c

RR
ht̄t contributes to

these relations at linear order in the SMEFT expansion. In particular,

cLLht̄t = cRR
ht̄t = − im

v
+ O

(
Λ−2

)
. (7.69)

It then follows that

icRRR
gt̄t = − 8v

Λ2
ReC33

uG, (7.70)

which, as expected, is a purely BSM coefficient, since its leading contribution
already appears at order 1/Λ2.



Chapter 8

Conclusions

On-shell amplitude methods provide a compelling approach to study BSM
physics directly at the level of the amplitude for a given scattering process,
in an EFT framework. At tree level, a satisfactory description of this ap-
proach has been developed in recent years. However, a comparably systematic
bottom-up construction of model-independent one-loop amplitudes is still less
developed.

In this thesis, we successfully computed the leading-order Higgs production
via gluon fusion in the EFT expansion, without the need for a Lagrangian
to dictate the interaction rules. Since the amplitude approach requires the
helicities of the massless particles involved to be specified from the outset, we
focused on the all-positive gluon-helicity configuration. The main result has
been presented in Eq. (7.63). This expression considers a subset of the LO
contributing diagrams, namely the SM-like triangle diagrams of Fig. 7.1. For
a precise definition of all the parameters entering the amplitude, see Ch. 7.

The first part of this amplitude correctly reproduces the SM contribution
in the corresponding limit, while the remaining structures are genuinely BSM.
As a benchmark of the calculation, we matched our result onto its SMEFT
counterpart and found complete agreement with Ref. [60].

A natural extension of this work would be to consider the other two com-
plementary diagrams contributing to the LO amplitude for the process of
interest, namely diagrams (6) and (7) of Fig. A.1. This additional contribu-
tion would be particularly interesting because the BSM vertex is now a four-
point interaction and therefore contains both factorizable and non-factorizable
structures.

Another possible direction would be to consider HEFT as an alternative
effective description of new physics. Among other things, HEFT relaxes some
of the assumptions underlying SMEFT by allowing the Goldstone bosons and
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the physical Higgs boson not to belong to the same linearly transforming
SU(2) doublet.

Furthermore, one could focus on the study of multi-Higgs production pro-
cesses induced by gluon–gluon fusion. Although these processes are charac-
terized by small cross sections, the inclusion of one-loop corrections is well
motivated by ongoing experimental efforts to measure double-Higgs produc-
tion [64–66] and even triple-Higgs production [67,68].

Lastly, at the High-Luminosity Large Hadron Collider (HL-LHC), multi-
dimensional differential distributions will provide increasingly detailed infor-
mation on the kinematic structure of scattering processes. This may enhance
the sensitivity to observables probing helicity and polarization effects, as well
as spin correlations and quantum observables [12, 13]. In this context, the
amplitude method provides a particularly suitable framework, since it makes
the helicity and spin structure of the scattering process manifest and thereby
facilitates a more direct connection with suitably designed observables.



Appendix A

SMEFT conventions and Feyn-
man rules of interest

In this appendix, we set our notations for the definition of SMEFT La-
grangian following [20]. First, we briefly review the SM Lagrangian before
the occurrence spontaneous symmetry breaking, then we present the relevant
Feynman rules for the Higgs production via gluon fusion in the SMEFT frame-
work. Finally, we evaluate the LO contribution to its scattering amplitude,
using computational techniques.

A.1 The Standard Model

A quantum field theory describing elementary particles and their interac-
tions is specified by its gauge symmetry, its field content and, possibily, by
the pattern of spontaneous symmetry breaking. The Standard Model (SM)
is a renormalizable and anomaly-free gauge theory based on the symmetry
group

GSM = SU(3)c × SU(2)L × U(1)Y , (A.1)

where SU(3)c describes the strong interactions, while SU(2)L ×U(1)Y is the
gauge group of the electroweak sector. The corresponding gauge fields are
denoted by GA

µ , W
I
µ and Bµ, with A = 1, . . . , 8 and I = 1, 2, 3.

The matter fields are arranged into three generations, labeled by p =
1, 2, 3. In the gauge basis, the left-handed fermions transform as doublets of
SU(2)L,

l′Lp =

(
ν ′Lp
e′Lp

)
, q′αLp =

(
u′αLp
d′αLp

)
, (A.2)

whereas the right-handed fermions,

e′Rp, u′αRp, d′αRp, (A.3)
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SU(3)c SU(2)L U(1)Y

l′Lp =

ν ′Lp
e′Lp

 1 2 −1
2

e′Rp 1 1 −1

q′Lp =

u′Lp
d′Lp

 3 2 +1
6

u′Rp 3 1 +2
3

d′Rp 3 1 −1
3

φ =

φ+

φ0

 1 2 +1
2

φ̃ = iσ2φ
∗ =

 φ0∗

−φ−

 1 2 −1
2

Table A.1: Transformation properties of the Standard Model fields under SU(3)c ×
SU(2)L × U(1)Y , where p = 1, 2, 3 labels the fermion generations.

are singlets under SU(2)L. Here α = 1, 2, 3 is a colour index. Notice we have
used ‘primed’ notation for fermion fields, reserving the ‘unprimed’ symbols
for the physical mass eigenstates basis, where flavor space rotations have been
performed.

The scalar sector contains one complex SU(2)L doublet,

φj =

(
φ+

φ0

)
, (A.4)

whose conjugate doublet is defined as

φ̃ = iσ2φ
∗. (A.5)

We collect in Tab. A.1 the transformation properties of the SM fields under
SU(3)c × SU(2)L × U(1)Y we have just introduced.

The electric charge is related to the third component of weak isospin and
to the weak hypercharge through

Q = T 3 + Y. (A.6)

The gauge interactions are introduced through the covariant derivative

Dµ = ∂µ + ig′BµY + igW I
µT

I + igsG
A
µT

A, (A.7)

where g′, g and gs are the U(1)Y , SU(2)L and SU(3)c gauge couplings, re-
spectively.
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In the fundamental representations, the generators of SU(2)L and SU(3)c
respectively are

tI =
σI

2
, TA =

λA

2
, (A.8)

with σI the Pauli matrices and λA the Gell-Mann matrices [2]. These satisfy

[tI , tJ ] = i ϵIJKtK , [TA, TB] = i fABCTC , (A.9)

and are normalized as

Tr
(
tItJ

)
=

1

2
δIJ , Tr

(
TATB

)
=

1

2
δAB. (A.10)

The generators that do not act on a given representation are understood
to vanish.

With the convention adopted in Eq. (A.7), the field-strength tensors are
defined through the commutator of covariant derivatives and explicitly read

Bµν = ∂µBν − ∂νBµ, (A.11)

W I
µν = ∂µW

I
ν − ∂νW

I
µ − g ϵIJKW J

µW
K
ν , (A.12)

GA
µν = ∂µG

A
ν − ∂νG

A
µ − gsf

ABCGB
µG

C
ν . (A.13)

Notice that the non-Abelian terms in W I
µν and GA

µν are responsible for the
three- and four-gauge-boson self-interactions characteristic of Yang–Mills the-
ories.

Finally, the complete renormalizable SM Lagrangian can be written as

L
(4)
SM = − 1

4
GA

µνG
Aµν − 1

4
W I

µνW
Iµν − 1

4
BµνB

µν

+ (Dµφ)
†(Dµφ) +m2φ†φ− λ

2
(φ†φ)2

+ i
(
l′L /Dl

′
L + e′R /De

′
R + q′L /Dq

′
L + u′R /Du

′
R + d′R /Dd

′
R

)
−
(
l′LΓee

′
Rφ+ q′LΓuu

′
Rφ̃+ q′LΓdd

′
Rφ+ h.c.

)
. (A.14)

We can conveniently separate the different sectors as

L
(4)
SM = Lgauge + Lfermion + LHiggs + LYukawa. (A.15)

Here, the gauge kinetic terms describe the propagation and self-interactions
of the gauge bosons. The fermion kinetic terms contain both the free fermion
dynamics and their interactions with the gauge fields. Them scalar kinetic
term generates the interactions between the Higgs doublet and the electroweak
gauge bosons, while the Yukawa sector provides fermion masses and Higgs–
fermion interactions after electroweak symmetry breaking.

We refer to standard textbooks [1,2] for the realization of the electroweak
symmetry breaking and the transition to the mass basis.
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A.2 gg → h at leading order in SMEFT

The renormalizable Lagrangian in Eq. (A.14) contains all operators of
canonical dimension equal or smaller than four that are compatible with
the SM gauge symmetry and field content. It therefore provides the natu-
ral dimension-4 starting point for the construction of SMEFT, namely

LSMEFT = LSM +
∑
d>4

L(d), L(d) =
∑
i

C
(d)
i

Λd−4
Q

(d)
i , (A.16)

where Q
(d)
i are gauge-invariant operators of dimension d, while C

(d)
i are the

corresponding Wilson coefficients.
The dimension-6 operators of interest for the process under study, namely

Higgs production via gluon fusion, are collected in Sec. 3.2 of the main text,
specifically in Eq. (3.16).

In this section, instead, we present the relevant Feynman rules that can
be obtained from those operators once spontaneous symmetry breaking has
been performed. The precise steps involved in the derivation are reported in
Ref. [20]. Conventionally, all momenta are taken to be incoming.

The direct Higgs–gluon interaction generated by QφG and Q
φG̃

is

h(p1)

gaµ(p2)

gbν(p3)

=
4iv

Λ2
δab
[
CφG (−p2 · p3 gµν + pν2p

µ
3 )

+ C
φG̃
ϵµνρσp2ρp3σ

]
.

(A.17)

The Higgs–top interaction is

h(p1)

t̄i(p2)

tj(p3)

= −iδji
mt

v

[
1 +

v2

Λ2

(
Cφ□ − 1

4
CφD

)]

+ iδji
v2√
2Λ2

[
Re
(
C33
uφ

)
+ i Im

(
C33
uφ

)
γ5
]
.

(A.18)
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The top–gluon interaction, including the chromomagnetic insertion, is

gaµ(p1)

t̄i(p2)

tj(p3)

= −igs(T a)jiγ
µ

−
√
2v

Λ2
pν1(T

a)ji σ
µν
[
Re
(
C33
uG

)
+ i Im

(
C33
uG

)
γ5
]
.

(A.19)
The chromomagnetic operator Q33

uG also generates the four-point interaction
ht̄tg,

h(p1)

gaµ(p2)
t̄i(p3)

tj(p4)

= −
√
2

Λ2
pν2(T

a)ji σ
µν
[
Re
(
C33
uG

)
+ i Im

(
C33
uG

)
γ5
]
.

(A.20)
Finally, the non-Abelian term in Ga

µν generates the contact vertices t̄tgg and
ht̄tgg. We omit these rules for brevity.

Notice that in the last three Feynman rules, we explicitly write the Wilson
coefficients C33

uϕ and C33
uG, splitting them into their real and imaginary parts.

This makes manifest the fact that the imaginary parts of these coefficients
are solely responsible for CP-odd interactions.

The Feynman rules reported in Eqs. (A.17), (A.18), (A.19), and (A.20)
are those contributing to the LO gg → h amplitude in SMEFT, in the 1/Λ2

expansion.

Having specified the rules of the model, we can proceed with the ex-
plicit computation of the amplitude. This is carried out with the aid of
SmeftFR v3.03 [18–20], FeynArts [21], and FeynCalc [22–24]. In par-
ticular, SmeftFR provides the Feynman rules for the process under con-
sideration, while FeynArts is used to generate the relevant diagrams and
amplitudes, and FeynCalc is used to perform the subsequent algebraic ma-
nipulations and loop reduction. The combined use of these three packages
therefore provides a complete framework for the automated evaluation of the
SMEFT amplitude.
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A.2.1 Computational implementation

To evaluate the SMEFT amplitude for the process gg → h at LO, we start
by choosing the following kinematic configuration

g(p1) + g(p2) → h(p). (A.21)

Then, by exploiting the CreateTopologies function of FeynArts the rele-
vant diagrammatic topologies can be generated. The corresponding particle
content is subsequently inserted through InsertFields, using the SMEFT
model file employed throughout this work. The relevant amplitudes are then
constructed with CreateFeynAmp. Schematically, this procedure takes the
form

topsLoop = CreateTopologies[1, 2 -> 1,

ExcludeTopologies -> {SelfEnergies, Tadpoles}];

insLoop = InsertFields[topsLoop,

{V[4], V[4]} -> {S[1]},

Model -> "SMEFTHgg",

GenericModel -> "SMEFTHgg",

InsertionLevel -> {Particles}];

ampLoopFA = CreateFeynAmp[insLoop, Truncated -> True];

The amplitudes generated by FeynArts are then converted into the internal
FeynCalc representation by means of FCFAConvert. In this step we denote
the loop momentum by k and perform the calculation in D dimensions. In
particular, the conversion is performed according to the schematic code

ampLoop = FCFAConvert[ampLoopFA,

IncomingMomenta -> {p1, p2},

OutgoingMomenta -> {p},

LoopMomenta -> {k},

ChangeDimension -> D,

UndoChiralSplittings -> True,

DropSumOver -> True,

Contract -> True,

TransversePolarizationVectors -> {p1, p2}];

An important step involves the evaluation of the traces. To this end,
we employ the NDR-Discard prescription [61]. In this prescription, traces
containing an unpaired γ5 are discarded, thus restricting the present analysis
to the CP-even part of the amplitude, as done in Ref. [25]. We note that
traces containing an odd number of γ5 matrices and six or more Dirac matrices
require particular care in dimensional regularization, due to the well-known
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reading-point ambiguity of the NDR scheme [69]. Since the corresponding CP-
odd contributions are not considered in the present calculation, this ambiguity
does not affect our result.

Furthermore, since the SMEFT amplitude is required only up to O(1/Λ2),
all Wilson coefficients are multiplied by an auxiliary parameter ϵWC and the
resulting expression is expanded up to first order,

Ci −→ ϵWCCi, M = MSM + ϵWCMdim-6 + O(ϵ2WC). (A.22)

The auxiliary parameter is set to one only after the truncation. This proce-
dure guarantees that products of dimension-6 Wilson coefficients, correspond-
ing to terms beyond the linear SMEFT approximation considered here, are
discarded. In Fig. A.1, we report the only contributing diagrams. Apart
from the pure SM contribution shown in diagram (2), all the other diagrams
contain one insertion each of a dimension-6 operator.

The resulting tensor loop integrals are reduced to the Passarino–Veltman
basis (see Ch. 6.1.2) using the TID function,

ampPV = TID[ampLinear, k, ToPaVe -> True];

so that the result could be expressed in terms of the scalar functions B0 and
C0, defined as

B0(p;m
2
1,m

2
2) ≡

∫
ddk

(2π)d
µ2ϵ(

k2 −m2
1

) [
(k + p)2 −m2

2

] ,
C0(p1, p2;m

2
1,m

2
2,m

2
3) ≡

∫
ddk

(2π)d
µ2ϵ(

k2 −m2
1

) [
(k + p1)2 −m2

2

]
× 1[

(k + p1 + p2)2 −m2
3

] ,
(A.23)

where we are employing the definitions given in Eq. (6.7). Lorentz contrac-
tions and scalar-product simplifications were subsequently carried out using
Contract, ExpandScalarProduct and DiracSimplify.

As a non-trivial check of the calculation, gauge invariance was verified.
Denoting the tensor amplitude by Mµν , we explicitly checked that

p1µM
µν = 0, p2νM

µν = 0. (A.24)

These identities were verified algebraically with FeynCalc after the tensor
reduction.
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The non-exhaustive steps we have just sketched yield

MSMEFT =
δab

2π3/2Λ2m2
hv
ε1µε2ν [p

ν
1p

µ
2 − (p1 · p2)gµν ]

{
√
2 Re

(
C33
uG

)
mm2

hv
√
αs

×
[
16π2B0(p;m

2,m2) + 16π2B0(p1;m
2,m2)

+ 32π2m2C0(p1, p2;m
2,m2,m2)− i

]
+ 4

√
πmαsX

[
8π2(4m2 −m2

h)C0(p1, p2;m
2,m2,m2) + i

]
+ 8iπ3/2CφG,0m

2
hv

2

}
, (A.25)

where we have introduced the convenient combination

X = Cφ□mv
2 − 1

4
CφDmv

2 − 1√
2
Re
(
C33
uφ

)
v3 + Λ2m. (A.26)

The scalar integrals appearing in the amplitude can be written in the following
way [25]

B0(p;m
2,m2) =

i

16π2
Γ(1 + ϵ)

(
4πµ2

m2

)ϵ [
1

ϵ
+ 2− 2g(τ)

]
+ O(ϵ),

B0(p1;m
2,m2) =

i

16π2
Γ(1 + ϵ)

(
4πµ2

m2

)ϵ
1

ϵ
+ O(ϵ),

C0(p1, p2;m
2,m2,m2) = − i

16π2m2

τ

2
f(τ) + O(ϵ),

(A.27)
where τ ≡ 4m2/m2

h and the functions f(τ) and g(τ) read

f(τ) =


arcsin2

(
1√
τ

)
, τ ≥ 1,

−1

4

[
ln

(
1 +

√
1− τ

1−
√
1− τ

)
− iπ

]2
, τ < 1,

g(τ) =


√
τ − 1 arcsin

(
1√
τ

)
, τ ≥ 1,

√
1− τ

[
ln

(
1 +

√
1− τ

1−
√
1− τ

)
− iπ

]
, τ < 1.

(A.28)

With these definition we can rewrite Eq. (A.25) in the standard form

MSMEFT = i
αs

3πv
δab ε1µε2ν [p

ν
1p

µ
2 − (p1 · p2)gµν ]F (τ). (A.29)
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where, the form factor F (τ) reads

F (τ) = Γ(1 + ϵ)

(
4πµ2

m2

)ϵ [
ctF1(τ) + cg0F2(τ) + Re(ctg)

m2

v2
F30(τ)

]
, (A.30)

with

F1(τ) =
3

2
τ [1 + (1− τ)f(τ)] ,

F2(τ) = 12,

F30(τ) =
6

ϵ
+ 3 [1− τf(τ)− 2g(τ)] ,

(A.31)

and in our notation

ct =
X

Λ2m
, cg0 =

πv2

αsΛ2
CφG,0, Re(ctg) =

v3√
2παsmΛ2

Re
(
C33
uG

)
. (A.32)

The above expression of the amplitude precisely coincide with the known
result obtained in Ref. [25]. The different normalization of the Wilson coeffi-
cients simply derives from using different conventions.

As a last step we should apply the renormalization procedure. Notice that
the chromomagnetic form factor F30(τ) contains an ultraviolet divergence of
the form 1/ϵ. As discussed in Ref. [25], this divergence can be absorbed into
the renormalization of the coefficient cg. The bare coefficient is written as

cg0 = cg(µR) + δcg, (A.33)

where µR denotes the renormalization scale of cg and the MS counterterm is

δcg =
m2

2v2
Re(ctg)Γ(1 + ϵ)(4π)ϵ

(
−1

ϵ
− ln

µ2

µ2R

)
. (A.34)

This counterterm reflects the one-loop mixing of Q33
uG into QφG appearing in

the SMEFT renormalization-group equations [70].
Since F2(τ) = 12, the counterterm proportional to δcg contributes pre-

cisely to the same Lorentz structure as the chromomagnetic term. After
consistently expanding the dimensional-regularization factors to order ϵ0, the
subtraction acting on F30 yields

F3(τ) = 3

[
1− τf(τ)− 2g(τ) + 2 ln

µ2R
m2

]
. (A.35)

The 1/ϵ pole has thus completely disappeared, as expected.
The final renormalized form factor can therefore be written as

F (τ) = ctF1(τ) + cg(µR)F2(τ) + Re(ctg)
m2

v2
F3(τ). (A.36)
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Figure A.1: Leading-order contributions to gg → h in the SMEFT at linear order in
1/Λ2. Diagram (1) corresponds to the direct Higgs–gluon interaction generated by
QφG. Diagram (2) is the pure Standard Model contribution. Diagram (3) denotes
the SM-like top-loop contribution with a modified Higgs–top interaction, receiving
corrections from Q33

uφ, Qφ□, and QφD. Diagrams (4)–(7) arise from a single insertion
of the chromomagnetic operator Q33

uG. Standard Model vertices are left unmarked,
while green, magenta, and cyan dots denote the modified Higgs–top, chromomagnetic,
and direct Higgs–gluon interactions, respectively.



Appendix B

Representations of the Lorentz
group

In this Appendix we briefly review the finite-dimensional representations
of the Lorentz group in four spacetime dimensions following Ref. [3]. The
notation that we introduce here is extensively employed in the main text, in
particular in the spinor helicity formalism.

B.1 The Lorentz group

The Lorentz group can be defined as the group of transformations that
leave the Minkowski metric invariant,

Λρ
µΛ

σ
νgρσ = gµν , (B.1)

where we use the mostly negative convention gµν = diag{+1,−1,−1,−1}.
A generic field ϕA(x), where A denotes a generic Lorentz index, transforms
according to

U(Λ)−1ϕA(x)U(Λ) = LA
B(Λ)ϕB(Λ

−1x), (B.2)

where U(Λ) acts on the Hilbert space and LA
B(Λ) is a finite-dimensional

matrix acting on the Lorentz indices of the field. The matrices LA
B(Λ) form

a representation of the Lorentz group, since they satisfy the composition rule

LA
B(Λ′)LB

C(Λ) = LA
C(Λ′Λ). (B.3)

For an infinitesimal Lorentz transformation,

Λµ
ν = δµν + ωµ

ν , ωµν = −ωνµ, (B.4)

the corresponding operator acting on the Hilbert space can be written as

U(1 + ω) = 1 +
i

2
ωµνM

µν , (B.5)
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where Mµν are the generators of Lorentz transformations. They satisfy the
Lorentz algebra

[Mµν ,Mρσ] = i (gµρMνσ − gνρMµσ − gµσMνρ + gνσMµρ) . (B.6)

It is convenient to separate rotations and boosts. We define

Ji =
1

2
ϵijkM

jk, Ki =M i0, (B.7)

where Ji generate spatial rotations and Ki generate boosts. The Lorentz
algebra then becomes

[Ji, Jj ] = iϵijkJk, (B.8)

[Ji,Kj ] = iϵijkKk, (B.9)

[Ki,Kj ] = −iϵijkJk. (B.10)

The first commutation relation is the usual angular momentum algebra. The
presence of the minus sign in the boost commutator reflects the non-compact
nature of the Lorentz group.

The classification of finite-dimensional representations becomes simple if
we define the combinations

Ni =
1

2
(Ji − iKi) , N i =

1

2
(Ji + iKi) . (B.11)

Using the Lorentz algebra above, one finds

[Ni, Nj ] = iϵijkNk, (B.12)

[N i, N j ] = iϵijkNk, (B.13)

[Ni, N j ] = 0. (B.14)

Therefore, the Lorentz algebra is equivalent, after complexification, to two
independent SU(2) algebras,

so(1, 3)C ≃ su(2)L ⊕ su(2)R. (B.15)

As a consequence, an irreducible finite-dimensional representation of the Lorentz
algebra is labelled by two angular momenta,

(jL, jR), (B.16)

where jL and jR are integers or half-integers. The dimension of the represen-
tation is

dim(jL, jR) = (2jL + 1)(2jR + 1). (B.17)

Some important examples are reported in Tab. B.1.
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Lorentz representation Dimension Field type

(0, 0) 1 scalar representation(
1
2 , 0
)

2 left-handed Weyl spinor(
0, 12
)

2 right-handed Weyl spinor(
1
2 ,

1
2

)
4 Lorentz vector

Table B.1: Some basic finite-dimensional representations of the Lorentz group.

B.1.1 Left- and right-handed spinor fields

We denote the left-handed Weyl spinors with a left-handed spinor index
that takes on two possible values

ψa(x). (B.18)

Whereas, we indicated a right-handed Weyl spinor as

ψ†
ȧ(x), (B.19)

where in this case ȧ is a right-handed spinor. In particular, a right-handed
Weyl field is the hermitian conjugate of a field in the

(
1
2 , 0
)
representation,

thus we write
[ψa(x)]

† = ψ†
ȧ(x). (B.20)

Under a Lorentz transformations, these object behave in the following way

U(Λ)−1ψa(x)U(Λ) = La
b(Λ)ψb(Λ

−1x), (B.21)

U(Λ)−1ψ†
ȧ(x)U(Λ) = Rȧ

ḃ(Λ)ψ†
ḃ
(Λ−1x), (B.22)

where La
b and Rȧ

ḃ are matrices in the
(
1
2 , 0
)
and

(
0, 12
)
representations, re-

spectively.

We introduce another invariant symbol of the Lorentz group ϵab, such that

La
c(Λ)Lb

d(Λ)ϵcd = ϵab. (B.23)

Notice this behavior is similar to that of the Minkowski metric gµν as reported
in Eq. (B.1). In particular, as we use gµν to raise and lower vector indices, we
can then use ϵab to raise and lower left-handed spinor indices. Analogously,
we can define another invariant symbol whose indices run in the right-handed
field representation, namely ϵȧḃ, such that

Rȧ
ċ(Λ)Rḃ

ḋ(Λ)εċḋ = εȧḃ. (B.24)

These two-component Levi-Civita tensors are defined as

ϵab = −ϵab = ϵȧḃ = −ϵȧḃ =
(

0 1
−1 0

)
. (B.25)
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With this definition, we have

εabε
bc = δa

c, εabεbc = δac. (B.26)

We can straightforwardly define

ψa(x) ≡ εabψb(x), (B.27)

which implies that

ψa = εabψ
b = εabε

bcψc = δa
cψc, (B.28)

as expected. However, the antisymmetry of εab implies that one has to be
careful with minus signs. For example, the previous definition can be written
in different equivalent forms:

ψa = εabψb = −εbaψb = −ψbε
ba = ψbε

ab. (B.29)

We must also be careful about signs when contracting indices. For instance,

ψaχa = εabψbχa = −εbaψbχa = −ψbχ
b. (B.30)

Another invariant symbol is

σµaȧ = (δaȧ, σ⃗aȧ) , (B.31)

where I is the 2× 2 identity matrix, and

σ1 =

(
0 1
1 0

)
, σ2 =

(
0 −i
i 0

)
, σ3 =

(
1 0
0 −1

)
(B.32)

are the Pauli matrices. Similarly, we can also define

σ̄µ ȧa ≡ ϵacϵȧḋσµ
cḋ
, (B.33)

which yields

σ̄µ ȧa =
(
δȧa,−σ⃗ȧa

)
. (B.34)

These two objects satisfy the following useful relations

σµaȧσ̄
ḃb
µ = 2δa

bδȧ
ḃ, (B.35)

Tr(σ̄µσν) = (σ̄µ)ȧa (σν)aȧ = 2gµν . (B.36)

Also,

Tr
(
σ̄ασβσ̄γσδ

)
+Tr

(
σασ̄βσγ σ̄δ

)
= 4(gαβgγδ − gαγgβδ + gαδgβγ), (B.37)
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where

Tr
(
σ̄ασβσ̄γσδ

)
= 2(gαβgγδ − gαγgβδ + gαδgβγ + iϵαβγδ), (B.38)

and,

Tr
(
σασ̄βσγ σ̄δ

)
= 2(gαβgγδ − gαγgβδ + gαδgβγ − iϵαβγδ). (B.39)

These two equations implement the convention ϵ0123 = +1, as in Ref. [46].
This explains why the signs in front of the Levi–Civita tensors are reversed
with respect to the corresponding relations reported in Ref. [71].

Moreover, σµaȧ and σ̄µ ȧa can be casted in a 4× 4 matrix

γµ =

(
0 (σµ)aȧ

(σ̄µ)ȧa 0

)
, (B.40)

which is the chiral basis representation of the gamma matrices. In this basis
the fifth gamma matrix reads

γ5 ≡ iγ0γ1γ2γ3 =

(
−I2 0
0 I2

)
, (B.41)

which explicitly separates the two Weyl representations of the Lorentz group

by means of the projector operators PL ≡ 1−γ5

2 and PR ≡ 1+γ5

2 , namely

ψL = PLψ =

(
I2 0
0 0

)
ψ, ψR = PRψ =

(
0 0
0 I2

)
ψ. (B.42)
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Useful spinor relation. In this paragraph we show a useful relation which
is used in Sec. 5.1.1 when matching the on-shell tree-level amplitude hgg onto
SMEFT,

p1ρp2σε
+
µ (p1)ε

+
ν (p2)ϵ

µνρσ = − i

2
[12]2. (B.43)

We prove it by choosing the reference momenta r1 = p2 and r2 = p1 in the
definition of the polarization vectors in Eq. (4.60):

ϵµνρσ p
ρ
1p

σ
2 ε

+µ
1 (p1; p2) ε

+ν
2 (p2; p1)

= ϵµνρσ p
ρ
1p

σ
2

[1|σ̄µ|2⟩√
2 ⟨12⟩

[2|σ̄ν |1⟩√
2 ⟨21⟩

=
ϵµνρσ p

ρ
1p

σ
2

2⟨12⟩⟨21⟩
(
|1⟩b[1|ȧ

)
(σ̄µ)ȧa

(
|2⟩a[2|ḃ

)
(σ̄ν)ḃb

=
ϵµνρσ p

ρ
1p

σ
2

2⟨12⟩⟨21⟩
p1αp2β (σ

α)bȧ(σ̄
µ)ȧa(σβ)aḃ(σ̄

ν)ḃb

=
ϵµνρσ p

ρ
1p

σ
2

2⟨12⟩⟨21⟩
p1αp2β Tr

(
σασ̄µσβσ̄ν

)
= − i ϵ

αµβνϵµνρσ
⟨12⟩⟨21⟩

pρ1p
σ
2p1αp2β

= − i ϵ
µνβαϵµνρσ
⟨12⟩⟨21⟩

pρ1p
σ
2p1αp2β

=
2i

⟨12⟩⟨21⟩

(
δβρ δ

α
σ − δβσδ

α
ρ

)
pρ1p

σ
2p1αp2β

=
2i

⟨12⟩⟨21⟩
[
(p1 · p2)2 − p21p

2
2

]
=
i

2

⟨12⟩2[21]2

⟨12⟩⟨21⟩

= − i

2
[12]2.

(B.44)

In the fifth step, we used Eq. (B.39), whereas in the seventh step we employed
the contraction identity

ϵµνβαϵµνρσ = −2
(
δβρ δ

α
σ − δβσδ

α
ρ

)
. (B.45)
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B.2 Particles in quantum field theory

We now turn our attention to the application of Lorentz transformations
on particle states rather than field. After a brief introduction on what is
meant for a particle state in quantum field theory, we will define the so-called
little group of the Lorentz group.

In quantum field theory, elementary particles are described as irreducible
unitary representations of the Poincaré group, which augments Lorentz group
by taking into account space-time translations too. Since spacetime transla-
tions are generated by the four-momentum operator Pµ, it is convenient to
choose one-particle states that are simultaneous eigenstates of all components
of Pµ,

Pµ|p, σ⟩ = pµ|p, σ⟩. (B.46)

Here pµ labels the four-momentum of the state, while σ denotes any additional
quantum number needed to distinguish states with the same momentum.

The commutativity of the momentum generators,

[Pµ, P ν ] = 0, (B.47)

ensures that the four components of Pµ can be simultaneously diagonalized.
In addition, the operator P 2 = PµP

µ is a Casimir operator of the Poincaré
algebra; see, e.g., [72]. Therefore, the subspace of states with a fixed eigen-
value of P 2 is invariant under Poincaré transformations.

Indeed, let us define the subspace of states |ℓ⟩

Lm2 =
{
|ℓ⟩ : P 2|ℓ⟩ = m2|ℓ⟩

}
. (B.48)

Since P 2 = PµP
µ is a Casimir operator of the Poincaré algebra, it is invariant

under Poincaré transformations

[P 2, U ] = 0, (B.49)

where U is the infinite-dimensional unitary representation of the Poicaré group,
whose existence is assured by Wigner’s theorem [72]. Therefore, for any state
|ℓ⟩ ∈ Lm2 , one has

P 2 (U |ℓ⟩) = UP 2|ℓ⟩
= Um2|ℓ⟩
= m2 (U |ℓ⟩) . (B.50)

Thus U |ℓ⟩ is again an eigenstate of P 2 with the same eigenvalue m2, namely

U |ℓ⟩ ∈ Lm2 . (B.51)

Hence the subspace Lm2 is an invariant subspace of the space of physical states
under Poincaré transformations.
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This, however, does not guarantee apriori that the representation acting
on this invariant subspace is irreducible, and indeed it is usually reducible1.

Up to now, we are sure that the momentum of the particle should be
considered as a ”quantum number” of the particle state and that there may
also be others adding up to its characterization. Therefore, we define a particle
state via its momentum pµ and comprise in σ all other possible labels of the
state. Such a state |p, σ⟩ clearly satisfies

P 2|p, σ⟩ = m2|p, σ⟩. (B.52)

B.2.1 Little group

Let U(Λ) be the unitary operator associated with a Lorentz transformation
Λ. Once a reference state |k, σ⟩ has been chosen, we define a generic one-
particle state with momentum pµ as

|p, σ⟩ ≡ U(L(p; k)) |k, σ⟩. (B.53)

The label σ denotes the remaining degrees of freedom that are not fixed by
the momentum.

We can now ask how the state |p, σ⟩ transforms under a general Lorentz
transformation Λ. Using the definition above, we have

U(Λ)|p, σ⟩ = U(Λ)U(L(p; k)) |k, σ⟩
= U(L(Λp; k))U †(L(Λp; k))U(Λ)U(L(p; k)) |k, σ⟩
≡ U(L(Λp; k))U(W )|k, σ⟩, (B.54)

where we have defined

W (Λ, p; k) ≡ L−1(Λp; k)ΛL(p; k). (B.55)

This transformation belongs to the little group of kµ, since

W (Λ, p; k)k = L−1(Λp; k)ΛL(p; k)k

= L−1(Λp; k)Λp

= L−1(Λp; k)(Λp)

= k. (B.56)

Hence, W (Λ, p; k) does not change the reference momentum, so it can act
non-trivially on the internal label σ. We write this action as

U(W (Λ, p; k)) |k, σ⟩ = Dσ′σ(W (Λ, p; k)) |k, σ′⟩, (B.57)

where Dσ′σ(W ) is a finite-dimensional representation of the little group.

1At this point one would need to introduce another Casimir of the Poincaré group which
is the square of the Pauli-Lubanski opertor. For a complete discussion on the subject please
see [72].
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Substituting this into the transformation law gives

U(Λ)|p, σ⟩ = Dσ′σ(W (Λ, p; k))U(L(Λp; k)) |k, σ′⟩
= Dσ′σ(W (Λ, p; k)) |Λp, σ′⟩. (B.58)

Thus, under a Lorentz transformation, the momentum label transforms as
p→ Λp, while the remaining label σ transforms according to a representation
of the little group. This is the sense in which the little group classifies the
spin degrees of freedom of one-particle states.

InD spacetime dimensions, the little group for massive particles is SO(D−
1) [48]. For massless particles, the little group is the group of Euclidean
symmetries in (D− 2) dimensions, namely SO(D− 2) augmented by (D− 2)
translations [48]. Finite-dimensional representations require all states to have
vanishing eigenvalues under these translations, and hence the relevant little
group reduces to SO(D − 2).





Appendix C

Massive spinor conventions

This Appendix collects the relevant relations among massive spinors which
are omitted from the main text for brevity. We first introduce useful relations
of the formalism which are extensively used in calculations and then introduce
the high energy limit, along with the massive polarization vectors. In this
discussion we mainly follow Ref. [46].

C.1 Useful relations among massive spinors

In the massive spinor helicity formalism several useful bilinear forms can
be obtained by using the expressions of the momentum in terms of spinor
variables, Eq. (4.107), and the equations of motions, Eq. (4.111),

|pI⟩α ⟨pI |β = −mδβα, |pI ]α̇ [pI |β̇ = mδα̇
β̇
,

⟨pI |pJ⟩ = −mϵIJ , [pI |pJ ] = mϵIJ ,

⟨pI |pJ⟩ = mδIJ , [pI |pJ ] = −mδIJ ,

⟨pI |pJ⟩ = mϵIJ , [pI |pJ ] = −mϵIJ .

(C.1)

Moreover, as for the massless case, we use the following convention for
spinors of negative momentum

| − pI⟩ = −|pI⟩, | − pI ] = +|pI ]. (C.2)

Also, for real momenta, complex conjugation acts in the following way(
|pI⟩

)∗
= [pI |,

(
|p]I
)∗

= −⟨p|I , (C.3)

consistently with the wavefunctions definitions of Eq. (4.110).
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C.2 The high energy limit

Let pµ be a massive momentum satisfying p2 = m2. Choosing a reference
frame in which the spatial momentum is directed along the z-axis, we write

pµ = kµ + qµ, (C.4)

where

kµ =
E + p

2


1
0
0
1

 , qµ =
E − p

2


1
0
0
−1

 , p ≡ |p| =
√
E2 −m2.

(C.5)
Indeed,

pµ =


E
0
0
p

 , p2 = (k + q)2 = E2 − p2 = m2. (C.6)

Moreover, both kµ and qµ are null momenta:

k2 =

(
E + p

2

)2

−
(
E + p

2

)2

= 0, (C.7)

q2 =

(
E − p

2

)2

−
(
−E − p

2

)2

= 0. (C.8)

In the high-energy limit, E ≫ m, one finds

E + p = E

(
1 +

√
1− m2

E2

)
= 2E − m2

2E
+ O

(
m4

E3

)
−→ 2E, (C.9)

E − p = E

(
1−

√
1− m2

E2

)
=
m2

2E
+ O

(
m4

E3

)
−→ m2

2E
. (C.10)

Hence,

qµ −→ 0, kµ −→ pµ as m −→ 0. (C.11)

Let us now formalize the high energy limit in terms of spinor helicity
variables. First, the massive momentum can be written in bispinor form as

|pI⟩a[pI |ȧ = paȧ = kaȧ + qaȧ

= |k⟩a[k|ȧ + |q⟩a[q|ȧ, (C.12)

|pI ]ȧ⟨pI |a = p̄ȧa = kȧa + qȧa

= |k]ȧ⟨k|a + |q]ȧ⟨q|a. (C.13)
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Therefore, we must have that the massive spinors can be expanded in a basis
ζ±I of the two-dimensional little-group space:

|pI⟩a = |k⟩a ζ−I + |q⟩a ζ+I , (C.14)

[pI |ȧ = [k|ȧ ζ+I − [q|ȧ ζ−I . (C.15)

Here I = 1, 2 is an index in the fundamental representation of the massive
little group SU(2). For a particle of spin s, the corresponding wavefunction
carries 2s symmetrized little-group indices as explained in the main text.

An explicit choice of basis is

ζ+I =

(
1
0

)
, ζ−I =

(
0
1

)
. (C.16)

With these conventions we can verify that

ϵIJζ
+Iζ+J = 0, ϵIJζ

−Iζ−J = 0, (C.17)

ϵIJζ
+Iζ−J = −1, ϵIJζ

−Iζ+J = 1. (C.18)

As a consistency check we may use Eqs. (C.14) and (C.15), obtaining

paȧ = ϵIJ |pI⟩a[pJ |ȧ
= ϵIJ

(
|k⟩aζ−I + |q⟩aζ+I

) (
[k|ȧζ+J − [q|ȧζ−J

)
= ϵIJζ

−Iζ+J |k⟩a[k|ȧ − ϵIJζ
+Iζ−J |q⟩a[q|ȧ

= |k⟩a[k|ȧ + |q⟩a[q|ȧ. (C.19)

which correctly reproduces Eq. (C.12).

C.3 Massive polarization vectors

The polarization vector associated with a massive spin-one particle of mo-
mentum p and massm can be written in the massive spinor-helicity formalism
as [46]

εIJµ =
⟨pI |σµ|pJ ]√

2m
, or equivalently, εIJαα̇ =

√
2
|pI⟩α[pJ |α̇

m
. (C.20)

Here I, J = 1, 2 are indices in the fundamental representation of the massive
little group SU(2). We require symmetrization over these two indices, since
for a massive spin-one particle we select the symmetric triplet representation,
which contains the three physical polarization states. In particular, the three
independent components of the symmetric product of two little-group dou-
blets correspond to the two transverse polarization states and the longitudinal
one.
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More explicitly, the positive- and negative-helicity components are

ε+µ ≡ ε11µ =
⟨p1|σµ|p1]√

2m
, (C.21)

ε−µ ≡ ε22µ =
⟨p2|σµ|p2]√

2m
, (C.22)

whereas the longitudinal component is

ε0µ ≡ ε12µ = ε21µ =
⟨p1|σµ|p2] + ⟨p2|σµ|p1]

2m
. (C.23)

These polarization vectors obey the standard orthonormality relation

εiµ
(
εjµ
)∗

= −δij , i, j = +,−, 0. (C.24)

The sum over the three physical polarization states gives∑
i=+,−,0

εiµ
(
εiν
)∗

= −
(
gµν −

pµpν
m2

)
. (C.25)

This expression also coincides with the numerator of the propagator of a
massive vector boson in unitary gauge.

Massless limit. In the high-energy or massless limit, the two transverse
massive polarization vectors reduce to the corresponding massless polarization
vectors. Using the decomposition introduced in the previous sections, namely
Eqs. (C.14) and (C.15), the I = J = 1 component becomes

ε11aȧ =
√
2
|p1⟩a[p1|ȧ

m

=
√
2
|q⟩a[k|ȧ
m

m→0−−−−→
√
2
|r⟩a[p|ȧ
⟨pr⟩

≡ ε+aȧ. (C.26)

Similarly, for I = J = 2,

ε22aȧ =
√
2
|p2⟩a[p2|ȧ

m

= −
√
2
|k⟩a[q|ȧ
m

m→0−−−−→
√
2
|p⟩a[r|ȧ
[pr]

≡ ε−aȧ. (C.27)

The massless limit was taken as prescribed by Eq. (C.11), namely the mo-
mentum qµ vanishes as m2, while its associated spinors vanish linearly with
m; on the other hand, the momentum kµ simply becomes pµ. For the former
momentum, we introduced the reference spinors |r⟩ and |r] by writing

|q⟩a =
m

⟨kr⟩
|r⟩a, [q|ȧ =

m

[rk]
[r|ȧ = − m

[kr]
[r|ȧ, (C.28)
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in this way we retain the direction of the momentum q by using the reference
one r. Also we explicitly highlight the high energy behavior of this momentum
by introducing the massm. In this way the massless limitm→ 0 can be safely
taken and correctly reproduces the two massless polarization vectors reported
in Eq. (4.63), as expected.

Let us finally consider the longitudinal polarization. Using the decompo-
sition of the massive spinors introduced above, one finds

ε0µ =
⟨p1|σµ|p2] + ⟨p2|σµ|p1]

2m

=
−⟨q|σµ|q] + ⟨k|σµ|k]

2m
(C.29)

=
kµ − qµ
m

. (C.30)

Therefore, in the high-energy limit,

ε0µ =
pµ
m

+ O
(m
E

)
. (C.31)

Contrary to the two transverse polarization states, the longitudinal polar-
ization does not admit a finite massless limit. Indeed, a massless spin-one
particle possesses only the two physical helicity states h = ±1, and hence
there is no longitudinal polarization state in the massless theory. The singu-
lar behavior of ε0µ as m → 0 reflects this change in the particle’s little-group
representation.

C.4 Identity for an amplitude with two mas-
sive and one massless leg

In this section a relation which is needed in Sec. 5.1.3 is derived. In the
context of bootstrapping the t̄tg tree level amplitude, the following indepen-
dent structure emerges

[12]
⟨r|/p1|3]
⟨r3⟩

, (C.32)

which depends on a arbitrary reference vector r. Here, p1 and p2 are the
two massive momenta of anti-top and top quarks, respectively. The massless
momentum p3 is instead assigned to the gluon.

We start by making use of the Schouten identity introduced in Eq. (4.53).
Its analogous form for dotted spinors reads

|i][jk] + |j][ki] + |k][ij] = 0. (C.33)

Choosing
|i] = |1], |j] = |2], |k] = |3], (C.34)

we obtain
|3][12] = −|1][23]− |2][31]. (C.35)
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Multiplying Eq. (C.35) from the left by ⟨r|/p1, we find

⟨r|/p1|3] [12] = −⟨r|/p1|1] [23]− ⟨r|/p1|2] [31]
= mt⟨r1I⟩[32]− ⟨r|/p1|2] [31], (C.36)

where in the second line we used the massive Weyl equation /p1|1] = mt|1⟩,
together with [23] = −[32].

The second term can be further simplified by using momentum conserva-
tion,

p1 = −p2 − p3. (C.37)

Indeed,

−⟨r|/p1|2] [31] =
(
⟨r|/p2|2] + ⟨r|/p3|2]

)
[31]

= (mt⟨r2⟩+ ⟨r3⟩[32]) [31]
= mt⟨r2⟩[31] + ⟨r3⟩[31][32]. (C.38)

Combining Eqs. (C.36) and (C.38), we therefore obtain

[12] ⟨r|/p1|3] = mt⟨r1⟩[32] +mt⟨r2⟩[31] + ⟨r3⟩[31][32].

Finally, dividing by ⟨r3⟩ and suppressing the massive little-group indices
through the bold notation gives

[12]
⟨r|/p1|3]
⟨r3⟩

= mt
⟨r1⟩[32] + ⟨r2⟩[31]

⟨r3⟩
+ [13][23]. (C.39)



Appendix D

Explicit computations for hgg
at one loop

In this Appendix, we collect some non-trivial calculations involving both
massless and massive spinor-helicity relations, which we exploit in Ch. 7. The
aim is to obtain the full LO amplitude for the process of Higgs production
via gluon fusion using amplitude methods.

To benchmark the computation, we first compute the SM amplitude, pro-
viding two different procedures which eventually lead to the same result. Fur-
thermore, we introduce the loop-momentum parametrizations for the triple,
double, and single cuts, which we exploit in the generalized unitarity algo-
rithm discussed in Sec. 7.2.

Eventually, we display the relevant calculations involved in the BSM con-
tribution to the amplitude.

D.1 Computation of SM integrand

D.1.1 SM integrand–way 1

In Sec. 7.1 of the main text, we aim to find the complete SM expression
for the hgg process at one loop. In order to do so, we implement the lower-
point tree-level amplitudes that make up the two relevant Feynman diagrams
of Fig. 7.1. By doing so, we obtain Eq. (7.16), which we report here for
completeness:

A++(k) = − 2παsm

v
δab
(
[kL3 |kI ]− ⟨kL3 |kI⟩

)
× ε+µ (p2; p3)

(
−⟨k2,J |γµ|kI ] + ⟨kI |γµ|k2,J ]

)
× ε+ν (p3; p2)

(
−⟨k3,L|γν |kJ2 ] + ⟨kJ2 |γν |k3,L]

)
, (D.1)
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In this section we perform the explicit calculation of the eight resulting terms.
Eventually, we will obtain Eq. (7.18) of the main text. The calculation reads

[kI |kL3 ]⟨k2J |γµ|kI ]⟨k3L|γν |kJ2 ] = [kI |kL3 ]⟨k3L|γν |kJ2 ]⟨k2J |γµ|kI ]
= [kI |ȧ |kL3 ]ȧ ⟨k3L|b(σν)bċ|kJ2 ]ċ ⟨k2J |d(σµ)dė|kI ]ė

= k3,αk2,β |kI ]ė[kI |ȧ (σ̄α)ȧb(σν)bċ(σ̄β)ċd(σµ)dė

= mk3,αk2,β Tr
(
σ̄ασν σ̄βσµ

)
. (D.2)

−[kI |kL3 ]⟨k2J |γµ|kI ][k3L|γν |kJ2 ⟩ = −[kI |kL3 ][k3L|γν |kJ2 ⟩⟨k2J |γµ|kI ]

= −[kI |ȧ|kL3 ]ȧ[k3L|ḃ(σ̄
ν)ḃc|kJ2 ⟩c⟨k2J |d(σµ)dė|kI ]ė

= m2 [kI |ḃ(σ̄
ν)ḃd(σµ)dė|kI ]ė

= m2 |kI ]ė[kI |ḃ(σ̄
ν)ḃd(σµ)dė

= m3 (σ̄ν)ėd(σµ)dė

= m3 Tr (σ̄νσµ) . (D.3)

−[kI |kL3 ][k2J |γµ|kI⟩⟨k3L|γν |kJ2 ] = −[kI |kL3 ]⟨k3L|γν |kJ2 ][k2J |γµ|kI⟩

= −[kI |ȧ|kL3 ]ȧ⟨k3L|b(σν)bċ|kJ2 ]ċ[k2J |ḋ(σ̄
µ)ḋe|kI⟩e

= m [kI |ȧ k̄ȧb3 (σν)bḋ(σ̄
µ)ḋe|kI⟩e

= m |kI⟩e[kI |ȧ k̄ȧb3 (σν)bḋ(σ̄
µ)ḋe

= mkeȧ k̄
ȧb
3 (σν)bḋ(σ̄

µ)ḋe

= mkαk3,β (σ
α)eȧ(σ̄

β)ȧb(σν)bḋ(σ̄
µ)ḋe

= mkαk3,β Tr
(
σασ̄βσν σ̄µ

)
. (D.4)

[kI |kL3 ][k2J |γµ|kI⟩[k3L|γν |kJ2 ⟩ = [kI |kL3 ][k3L|γν |kJ2 ⟩[k2J |γµ|kI⟩

= [kI |ȧ|kL3 ]ȧ[k3L|ḃ(σ̄
ν)ḃc|kJ2 ⟩c[k2J |ḋ(σ̄

µ)ḋe|kI⟩e
= −mk2,α |kI⟩e[kI |ḃ(σ̄

ν)ḃc(σα)cḋ(σ̄
µ)ḋe

= mk2,αkβ Tr
(
σβσ̄νσασ̄µ

)
. (D.5)

−⟨kI |kL3 ⟩⟨k2J |γµ|kI ]⟨k3L|γν |kJ2 ] = −⟨kI |kL3 ⟩⟨k3L|γν |kJ2 ]⟨k2J |γµ|kI ]
= −⟨kI |a|kL3 ⟩a⟨k3L|b(σν)bċ|kJ2 ]ċ⟨k2J |d(σµ)dė|kI ]ė

= mk2,α ⟨kI |b(σν)bċ(σ̄α)ċd(σµ)dė|kI ]ė

= mk2,αkβ Tr
(
σ̄βσν σ̄ασµ

)
. (D.6)
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⟨kI |kL3 ⟩⟨k2J |γµ|kI ][k3L|γν |kJ2 ⟩ = ⟨kI |kL3 ⟩[k3L|γν |kJ2 ⟩⟨k2J |γµ|kI ]

= ⟨kI |a|kL3 ⟩a[k3L|ḃ(σ̄
ν)ḃc|kJ2 ⟩c⟨k2J |d(σµ)dė|kI ]ė

= mk3,αkβ Tr
(
σ̄βσασ̄νσµ

)
= mk3,βkα Tr

(
σ̄ασβσ̄νσµ

)
. (D.7)

⟨kI |kL3 ⟩[k2J |γµ|kI⟩⟨k3L|γν |kJ2 ] = ⟨kI |kL3 ⟩⟨k3L|γν |kJ2 ][k2J |γµ|kI⟩

= ⟨kI |a|kL3 ⟩a⟨k3L|b(σν)bċ|kJ2 ]ċ[k2J |ḋ(σ̄
µ)ḋe|kI⟩e

= m3 Tr (σν σ̄µ) . (D.8)

−⟨kI |kL3 ⟩[k2J |γµ|kI⟩[k3L|γν |kJ2 ⟩ = −⟨kI |kL3 ⟩[k3L|γν |kJ2 ⟩[k2J |γµ|kI⟩

= −⟨kI |a|kL3 ⟩a[k3L|ḃ(σ̄
ν)ḃc|kJ2 ⟩c[k2J |ḋ(σ̄

µ)ḋe|kI⟩e

= mk3,αk2,β Tr
(
σασ̄νσβσ̄µ

)
. (D.9)

In these equations we exploited the massive momentum spinor variables de-
fined in Eq. (4.107), as well as the relations contained in Eq. (C.1).

Applying these equations, we obtain

A++(k) = − 2παsm

v
δabε+µ (p2; p3) ε

+
ν (p3; p2)

×

{
m

[
Tr
(
σ̄ασν σ̄βσµ

)
+Tr

(
σασ̄νσβσ̄µ

)]
(k3,αk2,β + kαk2,β)

+m

[
Tr
(
σ̄ασβσ̄νσµ

)
+Tr

(
σασ̄βσν σ̄µ

)]
kαk3,β

+m3

[
Tr (σ̄νσµ) + Tr (σν σ̄µ)

]}
, (D.10)

which is Eq. (7.18) of the main text. After performing the traces using Form
[57–59], we contracted the indices using Eqs.(7.13) and (7.14), and performed
some spinor manipulations. The expression then reads

A++(k) = − 8παsm
2

v
δab
(
− [23]2

m2
H

){
− ⟨2|/k|2]−

(
m2 − k2

)
+
m2

H

2

+
2

m2
H

[2|/k|3⟩[3|/k|2⟩

}
, (D.11)

namely Eq. (7.21) of the main text. For a more detailed derivation of this
last part, see the main text.
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D.1.2 SM amplitude–way 2

In this section, we provide an alternative derivation of the integrand
A++(k) in Eq. (7.19). In the main text, we factor out the polarization vec-
tors ε+2 and ε+3 and make them explicit only at the end, when converting the
expression back to spinor-helicity variables. In this section, we instead use
the slashed polarization vectors defined in Eq. (4.63) from the outset. We
will obtain the same result as in the main text, but only after applying the
Schouten identity to one term.

We start from the integrand expression for the SM contribution, in which,
with respect to Eq. (7.16), the polarization vectors are contracted with the γ
matrices,

A++(k) = − 2παsm

v
δab
(
[kL3 |kI ]− ⟨kL3 |kI⟩

)
×
(
−⟨k2,J | /ε+2 |k

I ] + ⟨kI | /ε+2 |k2,J ]
)

×
(
−⟨k3,L| /ε+3 |k

J
2 ] + ⟨kJ2 | /ε+3 |k3,L]

)
=

4παsm

v
δab

[23]2

m4
h

(
[kL3 |kI ]− ⟨kL3 |kI⟩

)
×
(
−⟨k2,J |3⟩[2|kI ] + ⟨kI |3⟩[2|k2,J ]

)
×
(
−⟨k3,L|2⟩[3|kJ2 ] + ⟨kJ2 |2⟩[3|k3,L]

)
, (D.12)

As before, eight terms need to be evaluated. We report the explicit calculation
below

[2|kI ] [kI |kL3 ] ⟨k3L|2⟩ [3|k2J ] ⟨kJ2 |3⟩ = m [2|/k|2⟩ [3|/k2|3⟩
= m ([2|/k|2⟩ − [23]⟨32⟩) ([3|/k|3⟩ − [32]⟨23⟩)
= m

(
[2|/k|2⟩ −m2

H

) (
[3|/k|3⟩ −m2

H

)
.
(D.13)

−[kI |kL3 ] ⟨k2J |3⟩ [2|kI ] [k3L|3] ⟨2|kJ2 ⟩ = −m3[23]⟨32⟩
= −m3m2

H . (D.14)

−[3|kJ2 ] [k2J |2] ⟨k3L|2⟩ [kI |kL3 ] ⟨3|kI⟩ = −m[32] ⟨2| /k3/k|3⟩
= −m[32]

(
⟨2|/k/k|3⟩ − ⟨23⟩[3|/k|3⟩

)
= −m[32]

(
k2⟨23⟩ − ⟨23⟩[3|/k|3⟩

)
= −mm2

H

(
k2 − [3|/k|3⟩

)
. (D.15)

[kI |kL3 ] [k2J |2] ⟨3|kI⟩ [k3L|3] ⟨2|kJ2 ⟩ = m [3|/k|3⟩ [2|/k|2⟩.
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−⟨kI |kL3 ⟩ ⟨k2J |3⟩ [2|kI ] ⟨k3L|2⟩ [3|kJ2 ] = m [3|/k2|3⟩ [2|/k|2⟩
= m ([3|/k|3⟩ − [32]⟨23⟩) [2|/k|2⟩
= m

(
[3|/k|3⟩ −m2

H

)
[2|/k|2⟩. (D.16)

⟨kI |kL3 ⟩ ⟨k2J |3⟩ [2|kI ] [k3L|3] ⟨2|kJ2 ⟩ = −m [2|/k /k3|3⟩ ⟨32⟩
= −m ([2|/k/k|3⟩ − [2|/k|2⟩[23]) ⟨32⟩
= −m

(
k2[23]⟨32⟩ − [2|/k|2⟩[23]⟨32⟩

)
= −mm2

H

(
k2 − [2|/k|2⟩

)
. (D.17)

⟨kI |kL3 ⟩ [k2J |2] ⟨3|kI⟩ ⟨k3L|2⟩ [3|kJ2 ] = −m3[23]⟨32⟩
= −m3m2

H . (D.18)

−⟨kI |kL3 ⟩ [k2J |2] ⟨3|kI⟩ [k3L|3] ⟨2|kJ2 ⟩ = m [3|/k2|3⟩ [2|/k|2⟩
= m ([3|/k|3⟩ − [32]⟨23⟩) [2|/k|2⟩
= m

(
[3|/k|3⟩ −m2

H

)
[2|/k|2⟩. (D.19)

Hence, we end up with

A++(k) =
4παsm

v
δab

[23]2

m4
h

{
mm4

H + 4m [3|/k|3⟩[2|/k|2⟩

− 2m3m2
H − 2mk2m2

H − 2mm2
H [2|/k|2⟩

}
. (D.20)

Although this method is more straightforward than the one adopted in the
main text, notice that the result we found seems to differ from that of
Eq. (7.21). The above expression contains a term of the form [3|/k|3⟩[2|/k|2⟩,
whereas the one in the main text interchanges 2 and 3 in the following way:
[2|/k|3⟩[3|/k|2⟩. When performing the unitarity cuts, this difference is essential,
since in the former case we cannot recover the rational-term contribution.
Fortunately, these two forms are related by the following identity:
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[3|/k|3⟩ [2|/k|2⟩ = −[3|kI ] [kJ |2] ⟨kI |3⟩⟨kJ |2⟩
= − ([3|2] [kJ |kI ] + [3|kJ ] [kI |2]) ⟨kI |3⟩⟨kJ |2⟩ (Schouten)

= −[kJ |kI ] [32] ⟨kI |3⟩⟨kJ |2⟩ − [3|kJ ] ⟨kJ |2⟩[kI |2] ⟨kI |3⟩
= [32] ⟨2|kJ⟩[kJ |kI ]⟨kI |3⟩+ [3|/k|2⟩[2|/k|3⟩
= [32] ⟨2|/k/k|3⟩+ [3|/k|2⟩[2|/k|3⟩
= k2[32]⟨23⟩+ [3|/k|2⟩[2|/k|3⟩
= k2m2

H + [3|/k|2⟩[2|/k|3⟩, (D.21)

where, in the second step, we used the Schouten identity reported in Eq. (4.59).
Employing this relation and collecting a common factor of 2m, we obtain

A++(k) = − 8παsm
2

v
δab
(
− [23]2

m2
H

){
− ⟨2|/k|2]−

(
m2 − k2

)
+
m2

H

2

+
2

m2
H

[2|/k|3⟩[3|/k|2⟩

}
, (D.22)

which precisely coincides with Eq. (7.21). This not only benchmarks our
calculation, but also allows us to select one of the two methods. Since the
method presented here involves Schouten rearrangements that may obscure
important contributions, the one reported in the main text is preferable. For
this reason, when computing the complete BSM amplitude arising from the
two SM-like diagrams, we will follow a procedure similar to the one adopted in
the main text. In particular, the term [2|/k|3⟩[3|/k|2⟩ becomes of fundamental
importance for the evaluation of rational terms, see Sec. D.3.

D.2 Loop-momentum parametrization

To find the complete expression of the amplitude for the one-loop hgg
process, we exploit generalized unitarity. This requires cutting through the
internal propagators of the diagrams, which amounts to putting the particles
flowing through them on shell. Therefore, as implied by the cutting rule in
Eq. (6.44), each propagator denominator is replaced by a Dirac delta. As a
consequence, once a given set of propagators is cut, the loop momentum is
constrained by the corresponding on-shell conditions.

In this appendix, we collect the loop-momentum parametrizations that
solve these constraints for the different cuts used in the calculation. Rather
than displaying the derivation separately for each cut, we summarize the
results in terms of a common parametrization.
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The on-shell conditions associated with the four propagators are

d0 = 0 ⇐⇒ k2 = m2,

d1 = 0 ⇐⇒ (k − p2 − p3)
2 = m2,

d2 = 0 ⇐⇒ (k − p2)
2 = m2,

d3 = 0 ⇐⇒ (k − p3)
2 = m2.

(D.23)

Using the loop-momentum decomposition introduced in Eq. (7.32), we
choose throughout

c =
m2

h

[23]2
z, (D.24)

for convenience. Therefore, the momentum associated with a generic cut C

can be written as

kµC = a pµ2 + b pµ3 +
m2

h

[23]2
z ε+µ

2 + d ε+µ
3 + kϵ n

µ
ϵ . (D.25)

The corresponding spinor representation is given by

/kC = a (|2⟩[2|+ |2]⟨2|) + b (|3⟩[3|+ |3]⟨3|)

+
m2

h

[23]2
z

√
2

⟨23⟩
(|2]⟨3|+ |3⟩[2|)

+ d

√
2

⟨32⟩
(|3]⟨2|+ |2⟩[3|) + kϵ /nϵ.

(D.26)

The resulting parametrizations for the triple, double, and single cuts are col-
lected in Tab. D.1. The triple, double, and single cuts leave one, two, and
three free parameters, respectively.

D.3 Implementation of the generalized uni-
tarity algorithm for the b01 coefficient

In Sec. 7.2, we qualitatively explained the algorithm used to implement
generalized unitarity as a tool for reconstructing the one-loop hgg scattering
amplitude. Here, we provide the explicit derivation of the coefficient b01 as
an example. In particular, we first discuss the physical interpretation of the
corresponding double cut in terms of cut diagrams, and then perform the
actual computation required to extract the coefficient. As discussed in the
main text, the same algorithm was also implemented in Mathematica [26]
using the package SMaSH [27].

We evaluate the coefficient b01 in the SM for the helicity configuration in
which both gluons have positive helicity. The amplitude is

MSM
++ =

∫
dDk

(2π)D
µ2ϵ ISM++(k), (D.27)
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Cut C a b d k2
C

Triple cuts

012 1 0
m2 − k2ϵ

2z
m2

013 0 1
m2 − k2ϵ

2z
m2

Double cuts

01 x 1− x
m2 − k2ϵ + x(x− 1)m2

h

2z
m2

02 x 0
m2 − k2ϵ

2z
m2

03 0 y
m2 − k2ϵ

2z
m2

12 1 y
m2 − k2ϵ

2z
m2 + ym2

h

13 x 1
m2 − k2ϵ

2z
m2 + xm2

h

Single cuts

0 x y
m2 − k2ϵ −m2

hxy

2z
m2

1 x y
m2 − k2ϵ −m2

h(1− x)(1− y)

2z
m2 + (x+ y −

1)m2
h

2 x y
m2

hy(1− x) +m2 − k2ϵ
2z

m2 + ym2
h

3 x y
m2

hx(1− y) +m2 − k2ϵ
2z

m2 + xm2
h

Table D.1: Loop-momentum parametrizations for the triple, double, and single cuts.

Here, we have defined c =
m2

h

[23]2 z for all cuts. The free parameters x, y, and z are in

general complex, as the cut conditions are solved in complexified momentum space.
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with

ISM++(k) =
ASM

++(k)

d0d1d2
+

ÃSM
++(k)

d0d1d3
. (D.28)

The direct numerator ASM
++(k) and the inverted one ÃSM

++(k) were obtained in
Eqs. (7.21) and (7.22), respectively. We report them here again for complete-
ness:

ASM
++(k) = − 8παsm

2

v
δab
(
− [23]2

m2
h

){
− ⟨2|/k|2]−

(
m2 − k2

)
+
m2

h

2

+
2

m2
h

[2|/k|3⟩[3|/k|2⟩

}
,

(D.29)

and

ÃSM
++(k) = − 8παsm

2

v
δab
(
− [32]2

m2
h

){
− ⟨3|/k|3]−

(
m2 − k2

)
+
m2

h

2

+
2

m2
h

[3|/k|2⟩[2|/k|3⟩

}
.

(D.30)

D.3.1 Physical interpretation of the double cut (01)

Before performing the explicit computation, it is useful to consider the
physical meaning of the double cut through propagators 0 and 1. This cut
does not isolate the bubble coefficient directly, since the same two propagators
also belong to both triangle topologies contributing to the physical amplitude.
Therefore, in order to extract b01, the higher-topology contributions already
determined from the triple cuts must first be subtracted.

Diagrammatically, the corresponding cut equation takes the form

1

2

3

0

1

2 + 1

3

2

0

1

3

− T012
1

2

3

0

1

2 − T013
1

3

2

0

1

3

= b01
1

2

3

0

1
.

(D.31)
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Here, T012 and T013 denote the complete D-dimensional residues associated
with the triple cuts (012) and (013), respectively. In terms of the notation used
in the scalar-integral decomposition, they contain both the four-dimensional
triangle coefficient and its k2ϵ -dependent part,

T012 = c012 +R012, T013 = c013 +R013. (D.32)

These coefficients are reported in Tab. (7.1) and read

T012 = T013 = δab
(
− [23]2

m2
h

)
4πm2αs

v

(
4m2 −m2

h − 4k2ϵ
)
, (D.33)

This distinction is useful here because the full D-dimensional residue must be
subtracted before the lower-topology coefficient can be isolated.

Using the explicit form of the integrands in Eq. (D.28), the diagrammatic
relation (D.31) becomes

∫
dDk

(2π)D
µ2ϵ

[
ASM

++(k)− T012
d2

+
ÃSM

++(k)− T013
d3

]
(−2iπ)2δ(d0)δ(d1)

= b01

∫
dDk

(2π)D
µ2ϵ(−2iπ)2δ(d0)δ(d1).

(D.34)

Since the cut measure is common to both sides, the bubble coefficient is
therefore obtained from

b01 =

[
ASM

++(k)− T012
d2

+
ÃSM

++(k)− T013
d3

]∣∣∣∣∣
d0=d1=0

. (D.35)

D.3.2 Explicit evaluation

We now evaluate Eq. (D.35). The first step is to determine the loop
momentum compatible with the double-cut conditions

d0(k) = d1(k) = 0. (D.36)

To this end we use the general van Neerven–Vermaseren parametrization in-
troduced in Eq. D.26 and the coefficients for the cut C = 01 reported in
Tab. D.1. We obtain

/k01 = x (|2⟩[2|+ |2]⟨2|) + (1− x) (|3⟩[3|+ |3]⟨3|)

+
m2

h

[23]2
z

√
2

⟨23⟩
(|2]⟨3|+ |3⟩[2|)

+
m2 − k2ϵ + x(x− 1)m2

h

2z

√
2

⟨32⟩
(|3]⟨2|+ |2⟩[3|) + kϵ /nϵ,

(D.37)
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which represents the constrained momentum that can flow in the diagrams
cut through 0 and 1. Conversely, the two propagators that remain uncut are
easily obtained from this parametrization. Since

d2 = (k − p2)
2 −m2, d3 = (k − p3)

2 −m2, (D.38)

and k2 = m2 on the cut, we find

d2 = −2k01 · p2 = (x− 1)m2
h, (D.39)

d3 = −2k01 · p3 = −xm2
h. (D.40)

In particular,
d2 + d3 = −m2

h, d2d3 = x(1− x)m4
h. (D.41)

We now evaluate the spinor structures entering Eqs. (D.29) and (D.30).
From Eq. (D.37), one immediately obtains

⟨2|/k01|2] = −d2, ⟨3|/k01|3] = −d3. (D.42)

Moreover, using the standard spinor identities and the explicit transverse part
of the cut momentum,

[2|/k01|3⟩[3|/k01|2⟩ = m2
h

[
k2ϵ −m2 − x(x− 1)m2

h

]
. (D.43)

The same expression is obtained after exchanging 2 ↔ 3.
Hence, using k201 = m2, the direct numerator becomes

ASM
++(k01) = − 8παsm

2

v
δab
(
− [23]2

m2
h

)
×

[
d2 +

m2
h

2
+ 2k2ϵ − 2m2 − 2x(x− 1)m2

h

]
, (D.44)

while for the inverted contribution we obtain

ÃSM
++(k01) = − 8παsm

2

v
δab
(
− [23]2

m2
h

)
×

[
d3 +

m2
h

2
+ 2k2ϵ − 2m2 − 2x(x− 1)m2

h

]
. (D.45)

Subtracting Eq. (D.33) from the two numerators gives

ASM
++(k01)− T012 = −8παsm

2

v
δab
(
− [23]2

m2
h

)[
d2 − 2x(x− 1)m2

h

]
, (D.46)

ÃSM
++(k01)− T013 = −8παsm

2

v
δab
(
− [23]2

m2
h

)[
d3 − 2x(x− 1)m2

h

]
. (D.47)
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Equation (D.35) therefore becomes

b01 = − 8παsm
2

v
δab
(
− [23]2

m2
h

)[
d2 − 2x(x− 1)m2

h

d2
+
d3 − 2x(x− 1)m2

h

d3

]
= − 8παsm

2

v
δab
(
− [23]2

m2
h

)[
2− 2x(x− 1)m2

h

(
1

d2
+

1

d3

)]
= − 8παsm

2

v
δab
(
− [23]2

m2
h

)[
2− 2x(x− 1)m2

h

(
− 1

x(1− x)m2
h

)]
= 0 (D.48)

The vanishing of b01 therefore results from a cancellation between the
direct and inverted triangle contributions after the higher-topology residues
have been subtracted. This provides a useful illustration of the top-down na-
ture of the generalized-unitarity reconstruction: the double cut alone does not
directly determine the bubble coefficient, but does so only once the informa-
tion obtained from the triple cuts has been removed. The same procedure is
applied to the remaining double and single cuts in the complete reconstruction
of the amplitude.
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D.4 Computation of BSM integrand

In Sec. 7.4.2 of the main text, we perform the calculation of the pure BSM
contribution in Eq. (7.57), which we report here for completeness:

A
cRRR
gt̄t

++ (k) = − i
δab

2
cgt̄t c

RRR
gt̄t

1

2
√
2
ε+2,µ ε

+
3,ν

(
cLLhtt̄⟨k

L
3 |kI⟩ − cRR

htt̄ [k
L
3 |kI ]

)
×

{(
⟨kI |γµ|k2,J ]− ⟨k2,J |γµ|kI ]

)
×
(
[kJ2 |3] ⟨3|γν |k3,L] + [k3,L|3] ⟨3|γν |kJ2 ]

)
+
(
[kI |2] ⟨2|γµ|k2,J ] + [k2,J |2] ⟨2|γµ|kI ]

)
×
(
⟨kJ2 |γν |k3,L]− ⟨k3,L|γν |kJ2 ]

)}
. (D.49)

Similarly to the procedure adopted in the SM case, we want to perform
the calculation in such a way as to single out the dependence on the loop
momentum k. Hence, the sixteen resulting terms are evaluated as follows:

[2|kI ] [kI |kL3 ] ⟨k3L|γν |kJ2 ] [k2J |γµ|2⟩ = −m2k3,αp2,β Tr
[
PLγ

βγαγνγµ
]
.

(D.50)

−[2|kI ] [kI |kL3 ] [k3L|γν |kJ2 ⟩ ⟨k2J |γµ|2⟩ = −m2k2,γp2,β Tr
[
PLγ

βγνγγγµ
]
.

(D.51)

−[2|k2J ] [kJ2 |γν |k3L⟩ [kL3 |kI ] [kI |γµ|2⟩ = m2k3,αp2,β Tr
[
PLγ

βγνγαγµ
]
.

(D.52)

[2|k2J ] ⟨kJ2 |γν |k3L] [kL3 |kI ] [kI |γµ|2⟩ = m2k2,γp2,β Tr
[
PLγ

βγγγνγµ
]
. (D.53)

−[2|kI ] ⟨kI |kL3 ⟩ ⟨k3L|γν |kJ2 ] [k2J |γµ|2⟩ = −m2kδp2,β Tr
[
PLγ

βγδγνγµ
]
.

(D.54)

[2|kI ] ⟨kI |kL3 ⟩ [k3L|γν |kJ2 ⟩ [k2J |γµ|2⟩ = −kδk3,αk2,γp2,β Tr
[
PLγ

βγδγαγνγγγµ
]
.

[2|k2J ] [kJ2 |γν |k3L⟩ ⟨kL3 |kI⟩ [kI |γµ|2⟩ = m2kδp2,β Tr
[
PLγ

βγνγδγµ
]
. (D.55)
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−[2|k2J ] ⟨kJ2 |γν |k3L] ⟨kL3 |kI⟩ [kI |γµ|2⟩

= kδk2,γk3,αp2,β Tr
[
PLγ

βγγγνγαγδγµ
]
. (D.56)

[3|kJ2 ] ⟨k2J |γµ|kI ] ⟨kI |kL3 ⟩ [k3L|γν |3⟩
= −m2k2,γ [3|γγγµγν |3⟩
= −m2k2,γp3,ρ Tr [PLγ

ργγγµγν ] . (D.57)

[3|k3L] [kL3 |kI ] [kI |γµ|k2J⟩ [kJ2 |γν |3⟩
= −m2k2,δ [3|γµγδγν |3⟩

= −m2k2,δp3,ρ Tr
[
PLγ

ργµγδγν
]
. (D.58)

−[3|kJ2 ] [k2J |γµ|kI⟩ [kI |kL3 ] [k3L|γν |3⟩
= −m2kδ [3|γµγδγν |3⟩

= −m2kδp3,ρ Tr
[
PLγ

ργµγδγν
]
. (D.59)

−[3|k3L] [kL3 |kI ] ⟨kI |γµ|k2J ] [kJ2 |γν |3⟩
= −m2kδ [3|γδγµγν |3⟩

= −m2kδp3,ρ Tr
[
PLγ

ργδγµγν
]
. (D.60)

−[3|kJ2 ] ⟨k2J |γµ|kI ] ⟨kI |kL3 ⟩ [k3L|γν |3⟩
= −k2,γkδk3,α [3|γγγµγδγαγν |3⟩

= −k2,γkδk3,αp3,ρ Tr
[
PLγ

ργγγµγδγαγν
]
. (D.61)

−[3|k3L] ⟨kL3 |kI⟩ [kI |γµ|k2J⟩ [kJ2 |γν |3⟩

= −k2,γkδk3,αp3,ρ Tr
[
PLγ

ργαγδγµγγγν
]
. (D.62)

[3|kJ2 ] [k2J |γµ|kI⟩ ⟨kI |kL3 ⟩ [k3L|γν |3⟩ = −m2k3,αp3,ρ Tr[PLγ
ργµγαγν ] . (D.63)
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[3|k3L] ⟨kL3 |kI⟩ ⟨kI |γµ|k2J ] [kJ2 |γν |3⟩ = −m2k3,αp3,ρ Tr[PLγ
ργαγµγν ] . (D.64)

Notice also that the choice of globally factoring out the polarization vectors in
the amplitude of Eq. (D.49) closely follows the method adopted in Sec. D.1.1.
In this way, we managed to express the result in terms of traces of γ matrices.
We obtain

A
cRRR
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++ (k) = − i
δab

2
cgt̄t c

RRR
gt̄t
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2
√
2
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]
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] ]
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[
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PLγ
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]
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]

+m2kδp2,β Tr
[
PLγ
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[
PLγ

βγγγνγαγδγµ
]

− k2,γkδk3,αp3,ρ Tr
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]
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−m2k3,αp3,ρ Tr [PLγ
ργαγµγν ]

]}
. (D.65)

To evaluate the traces, we adopt the NDR-Discard scheme [61], in which
the γ5-odd traces are set to zero, thus retaining only the CP-even part of the
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BSM amplitude. Explicitly,

Tr[PL Γ]
NDR-discard

=
1

2
Tr[Γ] , (D.66)

with Γ generically denoting a product of an even number of γ matrices. Evalu-
ating the traces using Form [57–59], and using the contractions in Eqs. (7.13)
and (7.14), yields
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++ (k) = − i
δab

2
cgt̄t c

RRR
gt̄t

1

2
√
2

{
2m2m2

h c
RR
htt̄

[23]2

m2
h

− 8 (k · p2)(k · p3) cLLhtt̄
[23]2

m2
h

+ 4 (k · p2) k2 cLLhtt̄
[23]2

m2
h

− 4 (k · p2)m2 cLLhtt̄
[23]2

m2
h

− 8 (k · p2)2 cLLhtt̄
[23]2

m2
h

+ 2 k2m2
h c

LL
htt̄

[23]2

m2
h

− 4m2
h c

LL
htt̄

(
k · ε+2

)(
k · ε+3

)}
. (D.67)

Using Eqs. (4.39), (7.12), and (7.20), we can convert the amplitude into spinor
variables, obtaining

A
cRRR
gt̄t

++ (k) = i
cgt̄t c

RRR
gt̄t

2
√
2

δab
(
− [23]2

m2
h
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h c
RR
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[
− ⟨2|/k|2] [3|/k|3⟩+ ⟨2|/k|2]

(
k2 −m2

)
− ⟨2|/k|2]2 + k2m2

h + ⟨2|/k|3] ⟨3|/k|2]

]}
. (D.68)

This is precisely Eq. (7.58) of the main text.
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